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ABSTRACT OF THE DISSERTATION

ASPECTS OF QUANTUM FIELD THEORY

by

Yanyan Li

Doctor of Philosophy in Physics

University of California, Los Angeles, 2026

Professor Thomas Dumitrescu, Chair

This dissertation is a collection of work on several aspects of quantum field theory, including

the worldsheet dynamics of vortex strings, non-invertible symmetries and their holographic

realizations, and quantum field theory in non-integer spacetime dimensions.

In Chapter 2, we study string excitations and the effective worldsheet action of Abrikosov–

Nielsen–Olesen vortex strings in the four-dimensional Abelian Higgs model. We analyze

fluctuations around the vortex and determine the worldsheet spectrum. Interestingly, we find

a light dilaton in the type-I regime and a light axion in the type-II regime. By integrating

out the massive modes, we compute the O(K4) Wilson coefficients of the effective string

action and compare the resulting theory with flux-tube S-matrix bootstrap constraints and

Yang–Mills confining strings. We also discuss the implications of this comparison for the

dual superconductor picture of confinement.

In Chapter 3, we study non-invertible defects in two-dimensional SN orbifold CFTs. We

construct universal defects which do not depend on the details of the seed CFT and hence

exist in any orbifold CFT. Additionally, we investigate non-universal defects arising from

the topological defects of the seed CFT. We argue that there exist universal defects that are

non-trivial in the large-N limit, making them relevant for the AdS3/CFT2 correspondence.

We then focus on AdS3 × S3 × M4 with one unit of NS–NS flux and propose an explicit

ii



realization of these defects on the worldsheet. We also calculate the entanglement entropy

in symmetric orbifold CFTs in the presence of topological defects.

In Chapter 4, we revisit the old problem of analytically continuing quantum field theories

to fractional dimension d ∈ C. We observe that common theories such as QCD and QED

have branch cuts in the complex d plane. In particular, many operators in their low-energy

CFTs have OPEs and scaling dimensions that jump as a function of d.
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CHAPTER 1

Introduction

Understanding strongly coupled quantum field theories remains one of the central challenges

in theoretical physics. Many fundamental questions, including renormalization-group flows

and infrared phases, the fate of symmetries, and possible dualities, are difficult to answer

directly from the microscopic theory. A broad range of analytic and numerical approaches

provide complementary perspectives on strongly coupled systems. Among these, extended

objects provide a particularly useful probe. They are ubiquitous in quantum field theory,

and their rich structures offer important insights into strongly coupled and non-perturbative

phenomena. The problems studied in this dissertation focus in particular on the dynamics

of long strings and on topological defects as realizations of generalized symmetries, with

applications to confinement, holography, and duality. We also investigate quantum field

theory in non-integer spacetime dimensions as a complementary perspective.

We first turn to the worldsheet dynamics of long strings and their connection to confine-

ment, which we study in Chapter 2. A hallmark of confinement is the formation of flux tubes,

or confining strings, which at long distances behave as weakly coupled strings described by

effective string theory. A long-standing open question is whether such flux tubes admit a

UV-complete worldsheet description. While lattice simulations, integrability, and bootstrap

analyses have revealed rich structures, analytic control remains limited, motivating the study

of more tractable models.

In this spirit, the Abelian Higgs model provides a semiclassical laboratory for studying

the dynamics of long strings. Its Abrikosov–Nielsen–Olesen (ANO) vortex strings carry

quantized magnetic flux and can be studied semiclassically. At sufficiently low energies,

1



their worldsheet dynamics are described by the translational Nambu–Goldstone modes. The

leading dynamics are governed by the universal Nambu–Goto action, while higher-derivative

corrections contain model-dependent Wilson coefficients that encode information about the

underlying four-dimensional theory [9, 10].

We systematically study the effective string theory of ANO vortex strings in the four-

dimensional Abelian Higgs model. We analyze the fluctuation spectrum, including the trans-

lational zero modes and massive excitations such as the dilaton, axion, and higher-spin

modes, and determine their couplings to the translational Goldstone modes. By integrating

out the massive excitations, we derive their contributions to the first non-universal O(K4)

higher-curvature corrections to the effective string action.

The resulting Wilson coefficients place the Abelian Higgs model within the space allowed

by the flux-tube S-matrix bootstrap [3, 4, 11] and make it possible to compare its world-

sheet dynamics directly with expectations for Yang–Mills confining strings. Interestingly,

the analysis reveals an inversion relative to confining-string expectations: the light axion

appears in the repulsive type-II regime, while the attractive type-I regime contains a light

dilaton. This indicates that the minimal Abelian Higgs model is not a compelling dual de-

scription of Yang–Mills confining strings. At the same time, it provides a controlled setting

for studying effective string dynamics and develops a framework that can be generalized

to more complicated theories. This comparison clarifies the relation between ANO vortex

strings and Yang–Mills confining strings and motivates extending the analysis to softly bro-

ken Seiberg–Witten theory [12, 13], where the dual superconductor picture is realized more

directly.

We next turn to non-invertible symmetries and topological defects, which we study in

Chapter 3. In recent years, generalized and non-invertible symmetries have provided valuable

insights into the dynamics of quantum field theories [14–16]. At the core of these general-

izations is the realization of symmetries as extended topological operators. Unlike ordinary

symmetry operators, their fusion need not be group-like, leading to a richer algebraic struc-

ture and new constraints on quantum field theories. This naturally raises the question of

2



how such generalized symmetry structures are realized in holographic duals.

Symmetric orbifold CFTs provide a particularly useful setting for addressing these ques-

tions. They are constructed by taking N copies of a seed CFT and gauging the permutation

group SN [17]. Gauging this non-abelian symmetry gives rise to a universal class of non-

invertible topological defects whose existence does not depend on the detailed dynamics of

the seed theory. In addition, topological defects of the seed theory give rise to non-universal

defects in the orbifold theory.

Symmetric orbifold CFTs are also important in AdS3/CFT2. They exhibit large-N fac-

torization and, for suitable seed theories, admit a holographic description in terms of string

theory on AdS3 × S3 ×M4. In particular, the symmetric orbifold point is related to a ten-

sionless string background with one unit of NS–NS flux [18–21]. This makes it natural to ask

which non-invertible defects remain nontrivial at large N and whether they admit a direct

realization in the dual string theory.

We construct the universal defects and study their fusion properties, defect Hilbert spaces,

and Ward identities. We also investigate non-universal defects inherited from topological

defects of the seed theory. We identify universal defects that remain nontrivial at large N

and propose a worldsheet realization of them as topological defects in the dual tensionless

string theory. This provides a concrete setting for studying non-invertible symmetries in

holography. We also study entanglement entropy in symmetric orbifold CFTs in the presence

of both universal and non-universal topological defects, providing an additional observable

that probes their structure and a possible holographic observable.

We finally turn to quantum field theory in non-integer spacetime dimensions, which we

study in Chapter 4. Analytic continuation in the spacetime dimension is familiar from

dimensional regularization and the ϵ-expansion. More conceptually, it provides a way to

connect quantum field theories defined in different integer dimensions and to ask in what

sense they can be regarded as members of the same family.

A natural question is whether one can define a family of QFTs, labeled by d ∈ C, that

agrees with the corresponding theories at several distinct integer dimensions, rather than only
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in an infinitesimal neighborhood of a particular integer value of d. This question is interesting

both for practical reasons, such as dimensional regularization, and for understanding how

physical phenomena and operator data evolve as the spacetime dimension is varied.

In Chapter 4, we revisit this problem and show that even vector-like theories such as

QCD and QED encounter important subtleties. The main obstruction to a naive analytic

continuation is the existence of low-rank exceptions: identities that hold only at special

integer dimensions can cause correlation functions and operator data to change qualitatively

as d is varied. As a result, expressions that are analytic at generic d need not reproduce the

correct theory at low integer dimensions.

We study these effects explicitly in interacting gauge theories using large-Nf methods.

Low-rank isomorphisms can make operators that transform differently at generic d become

equivalent at special integer dimensions, allowing them to mix and leading to branch points

in the complex d plane. Consequently, there is in general no single analytic expression for an

operator dimension that reproduces the correct answer at every integer dimension. Instead,

the continuation naturally develops multiple analytic branches. In particular, we find that

common theories such as QCD and QED have branch cuts in the complex d plane, and that

scaling dimensions and OPE data can jump as functions of d.
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CHAPTER 2

Effective Action of Long Magnetic Vortex Strings

2.1 Review of Effective String Theory

Given a gapped 3+1d QFT, we consider the low-energy modes of an infinite, stable string

of tension T . The string is nearly straight, with a weakly-curved worldsheet relative to the

string scale,

ℓs =
1√
T
. (2.1.1)

A perfectly straight string spontaneously brakes the 3+1d Poincaré symmetry as follows,

ISO(3, 1) −→ ISO(1, 1)× SO(2) . (2.1.2)

Here ISO(1, 1) is the Poincaré symmetry along the 1+1d worldsheet, while SO(2) rotates

the plane transverse to the string. This leads to two massless Nambu–Goldstone bosons

(NGBs) on the worldsheet, which describe its transverse fluctuations. Generically, they are

the only massless excitations on the string,1 and their low-energy effective field theory on

the worldsheet is often referred to as effective string theory (see [9, 10] for a review). It

takes the form a suitable derivative expansion, constrained by locality and the symmetries

of the problem. The latter are conveniently described by viewing the worldsheet, with

coordinates σα(α = 0, 1), as an embedded, oriented surface Xµ(σ) in 3+1d spacetime:

• The global Poincaré symmetry acts on Xµ as it does on the 3+1d spacetime coordi-

nates.

1 Additional gapless bosons (fermions) naturally arise if the string spontaneously breaks additional con-
tinuous (super-) symmetries. They can also arise as a result of fine-tuning, e.g. at the BPS point of the
Abelian Higgs model to be discussed below.
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• Worldsheet diffeomorphisms, under whichXµ(σ) is as a scalar, are a gauge redundancy.

It is convenient to explicitly fix static gauge,

X0(σα) = σ0 , X3(σα) = σ1 , (2.1.3)

where the physical degrees of freedom are the two transverse NGBs,2

X i(σα) , i = 1, 2 . (2.1.4)

Effective string theory is naturally phrased in terms of the extrinsic geometry of the

worldsheet; the building blocks are the induced metric hαβ = h(αβ) and the extrinsic curva-

ture Ki
αβ = Ki

(αβ), whose covariant definitions are

hαβ ≡ ηµν ∂αX
µ∂βX

ν , (2.1.5)

Kµ
αβ ≡ ∇α∂βX

µ = Ki
αβn

µ
i . (2.1.6)

Here µ = 0, 1, 2, 3 are bulk Minkowski indices, and ηµν = +−−− is the Minkowski metric.

The nµi (i = 1, 2) are orthonormal vectors that frame the 2d normal bundle of the worldsheet.

Here ∇α denotes the worldsheet covariant derivative.

In static gauge, the induced metric only depends on derivatives of the physical transverse

NGBs in (2.1.4),

hαβ = ηαβ + ∂αX
i∂βXi = ηαβ − ∂αX

i∂βX
i , (2.1.7)

where ηαβ = diag(+,−) is the flat Minkowski metric on the world sheet, defined using the

same conventions as the bulk Minkowski metric ηµν = diag(+,−,−,−). Here we introduce

a convention that we use throughout the paper: whenever two repeated normal bundle

indices are in the same position, such as the two raised i indices in (2.1.7), they are summed

over i = 1, 2 without any minus signs from the spatial components of the metric. This serves

2 Throughout the paper we use lowercase Latin letters i, j, k, . . . = 1, 2 to denote normal bundle indices;
Greek letters α, β, γ, . . . = 0, 1 from the beginning of the alphabet to denote 1+1d worldsheet Lorentz indices;
and (only rarely) Greek letters µ, ν, . . . = 0, 1, 2, 3 from the middle of the alphabet for 3+1d Lorentz indices.
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to make all minus signs coming from our negative spatial metric convention explicit, rather

than hiding them in lowered indices such as Xi = −X i.

Following [9], we classify terms in the effective action by their weight, defined as the

number of derivatives minus the number of X-fields. Since any possible term in the action

has non-negative weight,3 the derivative expansion can be organized by increasing weight.

We will only discuss terms of weight zero, two, and four:4

• There is a unique weight zero term: it is the familiar Nambu-Goto action,

S
(0)
NG = −T

∫︂
d2σ

√
−h , (2.1.8)

where h ≡ det(hαβ). The leading-weight equations of motion that follow from it are

hαβ∇α∇βX
µ = hαβKµ

αβ = 0 . (2.1.9)

• At weight two, there are two independent invariants, 5

S(2) =

∫︂
d2σ

√
−h
(︁
cRR + cK2(Ki

αβh
αβ)2

)︁
. (2.1.10)

Here, R is the worldsheet Ricci scalar constructed out of hαβ. The Gauss-Bonnet

theorem implies that the Einstein–Hilbert term is topological in two dimensions and

therefore does not contribute to the (local) dynamics. Furthermore, the term (Ki
αβh

αβ)2

is proportional to the Nambu-Goto equations of motion (2.1.9) and can be removed by

a field redefinition, at the expense of generating higher-weight terms. Thus, there are

effectively no operators to consider at weight two, as emphasized in [9].

• The first nontrivial corrections arise at weight four,

S(4) =

∫︂
d2σ

√
−h
(︁
cK4Ki

αβK
αβjKi

γδK
γδj + cR2R2

)︁
, (2.1.11)

3 This follows from 3+1d translations, which act on the X-fields by constant shifts.

4 The symmetries of the problem do not allow terms with odd weight [9].

5 An alternative basis at weight two consists of Ki
αβK

iαβ and Kiα
α Kiβ

β . The Gauss–Codazzi equation
allows us to trade these operators for R and Ki

αβK
iαβ .
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where the coefficients cK4 and cR2 are model-dependent and encode information about

the ultraviolet (UV) completion. Note that, following the conventions spelled out

below (2.1.7), we sum the repeated indices in (2.1.11) i, j = 1, 2 without any signs.

2.1.1 Flux-tube S-matrix bootstrap

Having identified cR2 and cK4 as the first model dependent coefficients in the effective string

action, it is natural to ask which values are compatible with a consistent ultraviolet comple-

tion. The flux-tube S-matrix bootstrap constrains these coefficients by imposing unitarity,

crossing symmetry, and analyticity on the scattering amplitudes of the translational Gold-

stones [3, 4]. The resulting allowed region provides a parameter space in which different

microscopic realizations of effective strings may be identified and compared.

In the conventions of [3], the weight-four interactions are parametrized by the dimension-

less coefficients α3 and β3. They are related to the coefficients in Eq. (2.1.11) through the

following linear combinations, with cR2 and cK4 measured in units of 1/T

α3 =
1

8
T (2cR2 + 3cK4) , β3 = −1

8
T (2cR2 + cK4) . (2.1.12)

In this work, we focus on ANO strings in the Abelian Higgs model and compute the

Wilson coefficients cR2 and cK4 explicitly, allowing us to place the ANO strings in the (α3, β3)

bootstrap parameter space. We first show the result in this parameter space. Figure 2.6

shows the trajectory of the fundamental n = 1 string as the Abelian Higgs model parameter

β, defined in (2.2.4), is varied. In the following sections, we develop the mode analysis used

to compute these coefficients, and return to the physical interpretation of the trajectory in

Sec. 2.6.
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2.2 Abelian Higgs Model

2.2.1 Lagrangian, Vacuum Structure and Symmetries

We study the Abelian Higgs model (AHM) in four spacetime dimensions (+,−,−,−), de-

scribing a single complex scalar field ϕ, carrying unit charge under the gauge group U(1).

The action is given by

S =

∫︂
d4x

(︃
−1

4
FµνF

µν + (Dµϕ)
†Dµϕ− λ

4
(|ϕ|2 − v2)2

)︃
, (2.2.1)

where Dµ = ∂µ + ieAµ and Fµν = ∂µAν − ∂νAµ. The strength of the electromagnetic

coupling is given by e and λ denotes the strength of the scalar self-coupling. They are both

dimensionless constants. The scales in the theory are set by the dimensionful real constant

v. We study the theory with λ > 0, which ensures that the theory undergoes the Higgs

mechanism.

The Abelian Higgs model has a unique vacuum. In the infrared, at weak coupling, the

theory undergoes Higgs mechanism and the U(1) gauge group is Higgsed down to nothing.

The Higgs vacuum is trivial and gapped. The vacuum condition at weak coupling, upto

gauge transformations is given by,

Aµ = 0 , ϕ = v . (2.2.2)

The spectrum in the Higgs vacuum consists of a massive vector boson with mass mV and a

massive Higgs boson with mass mH , given by,

m2
V = 2e2v2 , m2

H = λv2 . (2.2.3)

We can define a unique dimensionless ratio β given by,

β =
m2
H

m2
V

=
λ

2e2
. (2.2.4)

It is standard to refer to the β < 1 parameter regime as the type-I regime and β > 1 as

the type-II regime. For the Abelian Higgs model under consideration, β = 1 is a special

point and is referred to as the Bogomol’nyi-Prasad-Sommerfield (BPS point) [22, 23]. We
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can show that the AHM at the BPS point is the bosonic part of a supersymmetric QED

theory [24].

The Abelian Higgs model enjoys a global U(1)(1)m one form symmetry [25] (the superscript

is to identify the symmetry as one-form). The subscript m denotes that the symmetry is

magnetic - the objects charged under the symmetry are ’t Hooft lines. The associated current

and the charge n are given by:

∗j(2)m =
ef (2)

2π
, n ≡ 1

2π

∫︂
Σxy

da ∈ Z . (2.2.5)

Due to compact nature of the global symmetry group, the charge n ∈ Z. Conservation of

current follows from the Bianchi identity. Finite tension string states are created by acting

the ’t Hooft line operator on the vacuum. Here, U(1)(1)m is unbroken in the Higgs vacuum

and the strings realize this vacuum at long distances.

2.2.2 Rescaling

It is convenient to rescale the fields according to

ϕ→ ϕ

e
, Aµ → 1

e
Aµ , ˜︁v = ev . (2.2.6)

Under this rescaling, the action becomes

S =
1

e2

∫︂
d4x

(︃
−1

4
FµνF

µν + (Dµϕ)
†Dµϕ− β

2
(|ϕ|2 − ˜︁v2)2)︃ . (2.2.7)

where Dµ = ∂µ+ iAµ and β is defined in (2.2.4). In what follows, we work with this rescaled

action (2.2.7) and set ˜︁v = 1. The characteristic mass scale of the theory is then ev, and any

dimensionful quantity can be restored by dimensional analysis in powers of ev.

This form of the action also makes manifest that the overall factor 1/e2 controls the

semiclassical expansion, so that e2 serves as the loop-counting parameter. After canonically

normalizing the fluctuations, interaction vertices carry positive powers of e; in general, an

n-point interaction is of order en−2.
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2.2.3 String construction

In any flux sector n, there can be many string configurations, but there would be a ground

state or lowest energy string expected to be the most stable one. In order to solve for this

minimum energy configuration, we need to study PDEs of the Lagrangian (2.2.7) subject to

the flux constraint (2.2.5). This can be done, however in this paper, we will be interested in

axially symmetric strings where the magnetic flux is collimated along the z−direction. This

is a very standard simplifying assumption and the PDEs simplify to solving ODEs. For a

recent review, see [26].

In this section, we briefly review axially symmetric finite tension strings charged un-

der U(1)(1)m . In the context of the AHM, these strings have been extensively studied in

literature. In a non relativistic setting, these string solutions were first discussed in [27]

and in a relativistic context in [28]. These string solutions are the Abrikosov-Nielsen-Oleson

(ANO) strings. For a comprehensive textbook treatment, see [29, 30] and references therein.

See [26] for a recent discussion and review.

While the background string solutions are essentially unchanged in a non relativistic

setting, Lorentz symmetry becomes important when formulating the low energy effective

action in the string worldsheet. For a cartoon of an axially symmetric string configuration,

see figure 2.1.

It is best to work in cylindrical coordinates (r, θ, z). Consider a string aligned along

the z-axis, carrying charge n (2.2.5) under U(1)(1)m , referred to as the n-string. Requirement

of rotational symmetry 6 requires that the string configuration is also static and extends

uniformly along the z−axis. The axially symmetric ANO n-string ansatz is given by :

ϕ(x) = f(r)einθ , Aθ = nα(r) , Ai = 0 (i = t, r, z) , f(r), α(r) : R≥0 → R . (2.2.8)

With this in mind, it makes more sense to talk about the string tension T , defined as the

energy per unit length of a string, rather than the energy E. They are related by E = TL,

6 For the ANO string, rotational symmetry refers to the preserved diagonal combination of a spatial
rotation around the z−axis and a compensating global gauge transformation.
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Figure 2.1: A schematic depiction of an axially symmetric ANO vortex carrying n−units

of conserved magnetic flux along the z−axis. The red arrow illustrates the winding of the

Higgs field around the vortex. Requiring finite tension fixes the winding number to be n,

matching the total magnetic flux carried by the string.

where L is the length of the string. Henceforth in the paper, we will solely talk about the

string tension. Additionally, note that only Aθ is activated and the string solution entails

magnetic flux F12 flowing in the z−direction.

The winding of the scalar field is directly correlated with n, the units of flux flowing

through the string. This is a consequence of the finite tension requirement. In addition to

this, finiteness also sets the boundary conditions for the fields at radial infinity, where the

string realizes the Higgs vacuum. Regularity of Aθ , ϕ sets the boundary conditions at the

origin. Together these imply the following boundary conditions:

f(0) = 0 , α(0) = 0 , f(∞) = 1 , α(∞) = −1 . (2.2.9)

Substituting the string ansatz into the Hamiltonian for the theory, gives us the following

expression for the tension of a string carrying n units of magnetic flux,

Tn = 2πv2
∫︂ ∞

0

drr

(︃
n2α′2

2r2
+ f ′2 +

f 2n2

r2
(1 + α)2 +

β

2
(f 2 − 1)2

)︃
. (2.2.10)
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Table 2.1: Fundamental string tension T1 (2.2.10) for 20 values of β in units of v = 1.

β String tension

0.1 4.0150

0.2 4.5610

0.3 4.9296

0.4 5.2159

0.5 5.4533

0.6 5.6576

0.7 5.8379

0.8 6.0000

0.9 6.1475

1 6.2832

β String tension

2 7.2681

3 7.9225

4 8.4232

5 8.8327

6 9.1811

7 9.4852

8 9.7558

9 9.9998

10 10.2223

To get the equations of motion governing the dynamics of f(r) , α(r), we extremize the

expression for the string tension (2.2.10), which yields:

f ′′ +
f ′

r
− n2(α + 1)2

r2
f − βf(f 2 − 1) = 0 , (2.2.11a)

α′′ − α′

r
− 2f 2(α + 1) = 0 . (2.2.11b)

These equations do not admit analytic solutions and need to be solved numerically[31].

Analytic solutions can be written down in the infinite flux limit [26]. Consequently, we

obtain the behaviour of ANO strings as parameters n , β are varied. We can substitute

these numerical solutions into (2.2.10) and obtain the tension of an n−string. For the

fundamental n = 1 string, the tension is tabulated in (2.1) for various values of β.

The BPS point β = 1 is special and the AHM can be embedded into an N = 1 theory

which admits 1/2−BPS strings. At this point, the following first order equations are true,

and in turn imply the full equations of motion (2.2.11),

n√
2r
α′ =

√︃
β

2
(f 2 − 1) , f ′ =

n

r
f(1 + α) . (2.2.12)
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The string tension at the BPS point, takes a simple form:

Tn = 2πv2n . (2.2.13)

For the AHM, the parameter β = m2
H/m

2
V governs the dynamics of the ANO strings. Its

most immediate physical consequence is the static interaction between two parallel strings

separated by a large distance. This interaction arises from the exchange of the two massive

fields of the theory: the Higgs scalar of mass mH , whose exchange is attractive, and the

massive vector of mass mV , whose exchange is repulsive. At separations large compared

to the string width, each field contributes a screened potential set by its mass, and the

interaction energy per unit length of two unit-winding strings takes the form

U(d) ≃ 1

2π

[︂
q2V K0(mV d) − q2SK0(mHd)

]︂
, mV d, mHd ≫ 1 , (2.2.14)

where K0 is the modified Bessel function and qV , qS > 0 are the magnetic and scalar charges

of a single string, fixed by the large-distance tails of the profiles α(r) and f(r).7 Because

K0(µd) ∼
√︁
π/2µd e−µd for large argument, the term with the lighter exchanged field is the

longer ranged and controls the sign of the force at large d. In the type-I regime (β < 1)

the Higgs is lighter than the vector, mH < mV , so the attractive scalar exchange dominates

and the strings attract. In the type-II regime (β > 1) the vector is lighter, mV < mH , the

repulsive exchange dominates, and the strings repel. At the BPS point β = 1 the two masses

coincide, mH = mV , and the first-order equations (2.2.12) relate the profiles so that the

charges are equal, qS = qV ; the attractive and repulsive contributions then cancel identically,

and the strings exert no force on one another at any separation. This vanishing of the static

force is the origin of the moduli space of static multi-string configurations at critical coupling.

See [29] for a textbook treatment.

The same competition controls the stability of an n-string with n > 1. The relevant

comparison is between a single string of winding n, with tension Tn, and the configuration

7 Explicitly, the profiles approach the vacuum as 1 − f(r) ∼ qS
2πK0(mHr) and n

(︁
1 + α(r)

)︁
∼

qV
2π mV rK1(mV r) at large r, which defines the two charges. The corresponding force per unit length is
F(d) = −U ′(d) = 1

2π

[︁
q2VmVK1(mV d)− q2SmHK1(mHd)

]︁
.
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of n unit strings infinitely separated from one another, whose total tension is nT1. The

sign of the binding energy Eb ≡ nT1 − Tn is dictated by the inter-string force. In the

type-I regime the strings attract, so they bind: it is energetically favorable for them to

coalesce, Tn < nT1, and the n-string is a genuine stable bound state–the minimum-tension

configuration carrying n units of flux. In the type-II regime the strings repel, so Tn > nT1,

and the n-string is unstable; it lowers its energy by splitting into n fundamental strings that

fly apart to infinity, leaving the competing configuration of tension nT1 < Tn. At the BPS

point the strings are free, the binding energy vanishes, and Tn = nT1, as follows from the

BPS tension (2.2.13); the n-string is then only marginally stable, sitting exactly at threshold,

where it can be deformed into separated strings at no cost.

These energetic statements have a direct counterpart in the worldsheet fluctuation spec-

trum of the n-string, analyzed in Section 2.4. The marginal directions at the BPS point ap-

pear there as massless zero modes–the moduli labeling the relative positions of the constituent

strings–whereas in the type-II regime these same modes acquire negative mass squared and

become tachyonic, the fluctuation-level signal of the decay of the n-string into its separated

constituents. Equivalently, in terms of the one-form symmetry U(1)(1)m under which the string

carries charge n, the n-string is a stable, below-threshold bound state in the type-I regime

and an unstable, above-threshold state in the type-II regime.

2.3 Perturbing the ANO String

At sufficiently long distances, the dynamics of an ANO string is captured by the Nambu-

Goldstone massless modes associated with its broken transverse translations (Also see sec-

tion 2.1). Fluctuations of the Higgs and gauge fields around the ANO string background

(reviewed in section 2.2), give rise to a richer worldsheet spectrum, which in addition to the

translational zero modes, also includes normalizable massive bound states localized on the

string, and continuum scattering states.

The purpose of this section is to identify this worldsheet spectrum around ANO strings
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for various values of the parameters λ , e , and n. We do this by expanding the scalar and

gauge fields around the classical ANO string background and diagonalizing the quadratic

fluctuation operator. The resulting transverse eigenfunctions can be normalizable, associ-

ated with localized excitations on the string worldsheet, or non-normalizable, associated

with scattering states are smoothly connected with the bulk spectrum . The corresponding

eigenvalues of these eigenfunctions gives the worldsheet masses of these excitations.

Concretely, we write

ϕ(x) = ˜︁ϕ(r, θ) + δϕ(x) , (2.3.1)

ϕ∗(x) = ˜︁ϕ∗(r, θ) + δϕ∗(x) , (2.3.2)

Aµ(x) = ˜︁Aµ(r, θ) + δAµ(x) , (2.3.3)

where tildes denote the background solution (2.2.8). Since the minimum energy rotationally

symmetric ANO string is static and extends uniformly along the z−direction, it is inde-

pendent of the worldsheet coordinates and hence, the dependence of a fluctuation on (t, z)

can be separated from its transverse profile. The fluctuation modes can therefore be chosen

with definite worldsheet momentum, reducing the four-dimensional problem to a transverse

eigenvalue problem in the (r, θ) plane.

Throughout this section, it is useful to use complex coordinates in the transverse plane,

x± =
1√
2
r e±iθ , A+ =

e−iθ√
2

(︂
Ar − i

Aθ
r

)︂
, A− =

eiθ√
2

(︂
Ar + i

Aθ
r

)︂
, (2.3.4)

so that A± carry definite transverse spin, just like ∂±. We use Cartesian coordinates

(t, x, y, z), cylindrical coordinates (t, r, θ, z), and complex transverse coordinates (t, x+, x−, z)

interchangeably. The ANO background gauge field then becomes

˜︁A+ = − i
nα√
2 r

e−iθ , ˜︁A− = i
nα√
2 r

eiθ . (2.3.5)

Before turning to the detailed derivation, we summarize the structure of the fluctuation

problem. A useful way to organize the fluctuations is to separate the components that

transform differently under the symmetries preserved by the string. The scalar fluctuation
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mixes with the transverse gauge-field components, while the gauge-field components along

the string form a separate channel:

Dilaton channel: δΨ(D) ≡

⎛⎜⎜⎜⎜⎜⎜⎝
δϕ

δϕ∗

δA+

δA−

⎞⎟⎟⎟⎟⎟⎟⎠ , Axion channel: δAα , (2.3.6)

where α ∈ {t, z} denotes the worldsheet directions. This terminology is motivated by the

worldsheet parity of the physical modes: after imposing the physical constraints, modes in

the dilaton channel are even under worldsheet parity, P∥ = +, while modes in the axion

channel are odd, P∥ = −. Thus the two channels correspond to the two worldsheet-parity

sectors of the fluctuation problem. The separation into these two channels follows from the

symmetries preserved by the string background, which we review in Sec. 2.3.1.

After gauge fixing, the physical fluctuation problem takes a simple form. The dilaton

channel is governed by a coupled operator acting on the scalar fluctuation and the transverse

gauge-field components,

D δΨ(D) = 0 , (2.3.7)

together with the gauge constraint (2.3.16). The axion channel is governed by the wave

equation for the worldsheet gauge-field components,

(︁
□+ 2|˜︁ϕ|2)︁ δAα = 0 , ∇αδAα = 0 . (2.3.8)

The role of these equations is to determine which four-dimensional fluctuations become

physical fields on the string. After separating the worldsheet dependence and decompos-

ing the transverse profiles into angular-momentum eigenmodes, the two channels reduce to

transverse eigenvalue problems,

D⊥χ
(D)
m,Nm

=
(︂
M

(D)
m,Nm

)︂2
χ
(D)
m,Nm

, (2.3.9)(︂
−∇2

i + 2|˜︁ϕ|2)︂χ(A)
m,Nm

=
(︂
M

(A)
m,Nm

)︂2
χ
(A)
m,Nm

. (2.3.10)
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Here m ∈ Z labels transverse spin, and Nm labels the radial excitation level in a fixed

spin sector. The eigenfunctions χm,Nm describe the transverse profiles of the modes, while

the eigenvalues Mm,Nm are their masses from the worldsheet point of view. Thus the four-

dimensional fluctuation problem becomes a classification of two-dimensional particles living

on the string: zero modes, possible massive bound states localized near the core, and con-

tinuum scattering states.

The rest of this section derives this structure systematically. In Sec. 2.3.1 we identify the

symmetries preserved by the ANO string and use them to classify the fluctuation modes. In

Sec. 2.3.2 we discuss the gauge choices needed to isolate the physical modes and derive the

quadratic action. We then solve the fluctuation problem in the dilaton channel in Sec. 2.3.3

and in the axion channel in Sec. 2.3.4.

2.3.1 Unbroken symmetries and quantum numbers

The fluctuation operator inherits the symmetries preserved by the ANO string background.

These symmetries organize the fluctuation modes into sectors labeled by transverse spin and

parity. This classification will be useful both for solving the transverse eigenvalue problem

and for identifying the resulting worldsheet particles.

The ANO string lies in a fixed sector of the magnetic one-form symmetry U(1)(1)m , labeled

by its flux n. Within this fixed-flux sector, the small fluctuations are classified by the

spacetime symmetries preserved by the straight string. These are

O(1, 1)∥ ×O(2)⊥ . (2.3.11)

The continuous part consists of the worldsheet Poincaré group ISO(1, 1) acting on (t, z)

and the transverse rotations SO(2)⊥. In addition, the background preserves two discrete

reflections. We now spell out the action of these symmetries on the fluctuation fields, since

these transformation laws determine the quantum numbers used throughout the spectrum

analysis.

• Transverse rotations SO(2)⊥. A rotation R(α) ∈ SO(2)⊥ acts as θ → θ + α
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and is accompanied by a compensating rigid U(1) gauge transformation under which˜︁ϕ → e−inα˜︁ϕ and ˜︁Aµ → ˜︁Aµ, leaving the background invariant. Under this combined

action the fluctuations transform as8⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

δϕ(θ)

δϕ∗(θ)

δA+(θ)

δA−(θ)

δAz(θ)

δA0(θ)

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠
↦−→

⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

e−inα

einα

eiα

e−iα

1

1

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠

⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

δϕ(θ + α)

δϕ∗(θ + α)

δA+(θ + α)

δA−(θ + α)

δAz(θ + α)

δA0(θ + α)

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠
. (2.3.12)

The generator of SO(2)⊥ is the transverse spin, which we denote by m ∈ Z.

• Transverse parity CRy. This transformation combines the spatial reflection y ↦→ −y

(equivalently θ ↦→ −θ) with complex conjugation of the fields. Under CRy,⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

δϕ(θ)

δϕ∗(θ)

δA+(θ)

δA−(θ)

δAz(θ)

δA0(θ)

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠
↦−→

⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

0 1

1 0

0 −1

−1 0

−1 0

0 −1

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠

⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

δϕ(−θ)

δϕ∗(−θ)

δA+(−θ)

δA−(−θ)

δAz(−θ)

δA0(−θ)

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠
. (2.3.13)

Its eigenvalues are P⊥ = ±1, denoting even and odd transverse parity. In what follows

we use P⊥ interchangeably for the operator CRy and for its eigenvalue, the meaning

being clear from context. This reflection exchanges the spin-m and spin-(−m) sectors.

• Worldsheet parity Rz. This is the reflection z ↦→ −z along the string axis, a

8 We display only the dependence on the angular coordinate θ, the sole coordinate affected by the SO(2)⊥
transformation; the fluctuations remain functions of all spacetime coordinates. Unspecified entries in the
transformation matrices vanish.
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worldsheet parity transformation. Under Rz,⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

δϕ(z)

δϕ∗(z)

δA+(z)

δA−(z)

δAz(z)

δA0(z)

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠
↦−→

⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

1

1

1

1

−1

1

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠

⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

δϕ(−z)

δϕ∗(−z)

δA+(−z)

δA−(−z)

δAz(−z)

δA0(−z)

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠
. (2.3.14)

Its eigenvalues are P∥ = ±1, denoting even and odd worldsheet parity; as with P⊥, we

use P∥ for both the operator and its eigenvalue.

We now translate these transformation laws into the labels used for the spectrum. The

transverse reflection does not commute with the rotations. Instead,

CRy R(α)CR
−1
y = R(−α) , (2.3.15)

so CRy maps a spin-m mode to a spin-(−m) mode. Therefore modes with m ̸= 0 arrange

into degenerate O(2)⊥ doublets {m,−m}. By contrast, the m = 0 modes are O(2)⊥ singlets

and can be chosen to have definite transverse parity P⊥.

Including the worldsheet parity, the m = 0 modes carry the quantum numbers 0P⊥P∥ . For

|m| ̸= 0, one may either work in a spin-diagonal basis and label the doublets by mP∥ , or in

a parity-diagonal basis and label them by |m|P⊥P∥ . Throughout, we take the representative

m > 0 of each doublet and write mP∥ , with the partner of spin −m obtained by acting with

P⊥.

This symmetry analysis explains the channel decomposition summarized above. As we

show in Sec. 2.3.2, the fluctuations (δϕ, δϕ∗, δA+, δA−) and δAα decouple: the former con-

stitute the dilaton channel and are even under worldsheet parity, P∥ = +, while the physical

modes of the latter constitute the axion channel and are odd, P∥ = −. Thus the fluctua-

tion problem splits into two independent worldsheet-parity sectors, which organize both the

eigenvalue problems solved below and the worldsheet spectrum analyzed in Sec. 2.4.
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2.3.2 Gauge fixing and the quadratic action

Gauge fixing plays an important role in the fluctuation analysis. Around the vortex back-

ground, the scalar and gauge-field fluctuations mix, and the gauge redundancy must be

removed before identifying the physical worldsheet modes. We will use two gauge choices,

adapted to different purposes. The unitary gauge makes the physical spectrum manifest and

will be used in the mode analysis below. The background gauge is more convenient for the

effective-action calculation in Sec. 2.5; it also matches the gauge choice commonly used in

fluctuation analyses of vortices, making contact with previous work more direct.

2.3.2.1 Unitary gauge

We first use a unitary gauge adapted to the vortex background. It is defined by the condition

∇iδAi + i˜︁ϕ∗δϕ− i˜︁ϕδϕ∗ = 0 , (2.3.16)

which fixes the gauge redundancy completely. Expanding the action about the ANO back-

ground in this gauge gives

SU = −Tn
∫︂
d2σ + S

(2)
U + S

(3)
U + S

(4)
U , (2.3.17)

with the quadratic part9

S
(2)
U =

1

2e2

∫︂
d4x

[︂
δΨ(D)†D δΨ(D) + δAα

(︂
□ + 2|˜︁ϕ|2 )︂ δAα + (∇αδAα)

2
]︂
, (2.3.18)

where the dilaton-channel fluctuation vector and its conjugate are

δΨ(D) =

⎛⎜⎜⎜⎜⎜⎜⎝
δϕ

δϕ∗

δA+

δA−

⎞⎟⎟⎟⎟⎟⎟⎠ , δΨ(D)† =
(︂
δϕ∗ δϕ δA− δA+

)︂
. (2.3.19)

9 The gauge-fixing condition holds for physical configurations and may equally be imposed off shell to
simplify the action.
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The quadratic fluctuation operator takes the form

D =

⎛⎜⎜⎜⎜⎜⎜⎝
O (1− β)˜︁ϕ2 2iD−˜︁ϕ 2iD+

˜︁ϕ
(1− β)˜︁ϕ∗2 O∗ −2iD−˜︁ϕ∗ −2iD+

˜︁ϕ∗

−2iD+
˜︁ϕ∗ 2iD+

˜︁ϕ −□− 2|˜︁ϕ|2 0

−2iD−˜︁ϕ∗ 2iD−˜︁ϕ 0 −□− 2|˜︁ϕ|2

⎞⎟⎟⎟⎟⎟⎟⎠ , (2.3.20)

where D±˜︁ϕ = (∂± + i ˜︁A±)˜︁ϕ and D±˜︁ϕ∗ = (∂± − i ˜︁A±)˜︁ϕ∗ are the background covariant deriva-

tives, and

O = −□+ 2i ˜︁Ai∂i − ˜︁Ai ˜︁Ai − β(2|˜︁ϕ|2 − 1)− |˜︁ϕ|2 . (2.3.21)

There are two important consequences of the quadratic action. First, the fluctuation

problem separates into the two channels introduced above. The four-component field δΨ(D)

and the worldsheet gauge components δAα do not mix in (2.3.18). This decoupling is the

dynamical realization of the symmetry decomposition discussed in Sec. 2.3.1.10

Second, the equations of motion must be supplemented by constraints that remove un-

physical gauge components. In the dilaton channel, the physical fluctuations are the solutions

of

D δΨ(D) = 0 , (2.3.22)

that also obey the gauge condition (2.3.16). In the axion channel, the physical modes obey an

additional transversality constraint. The linearized equation for δAα following from (2.3.18)

is

□δAα −∇α∇βδAβ + 2|˜︁ϕ|2δAα = 0 . (2.3.23)

Taking its worldsheet divergence yields(︂
−∇2

i + 2|˜︁ϕ|2)︂∇αδAα = 0 , (2.3.24)

10 By a channel we mean the decomposition into (δϕ, δϕ∗, δA+, δA−) and δAα; by a sector we mean the
further classification by spin within a channel.
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and since the operator −∇2
i + 2|˜︁ϕ|2 is positive it has only the trivial kernel, giving the

constraint

∇αδAα = 0 . (2.3.25)

Substituting this back into the linearized equation reduces it to the wave equation

(□+ 2|˜︁ϕ|2)δAα = 0 . (2.3.26)

Thus the physical dilaton modes solve (2.3.22) subject to (2.3.16), while the physical axion

modes solve (2.3.26) subject to (2.3.25).

The cubic and quartic terms in SU encode the interactions among the fluctuations,

S
(3)
U =

1

e2

∫︂
d4x

[︁
− i δAµ δϕ

∗∇µδϕ+ δAµ δA
µ δϕ∗ ˜︁ϕ

+ ˜︁Aµ δAµ δϕ∗ δϕ− β δϕ δϕ δϕ∗ ˜︁ϕ∗]︁+ h.c. , (2.3.27)

S
(4)
U =

1

e2

∫︂
d4x

(︃
δAµ δA

µ δϕ δϕ∗ − 1

2
β δϕ2 (δϕ∗)2

)︃
, (2.3.28)

where “h.c.” denotes the Hermitian conjugate of the preceding terms. These interaction terms

do not affect the linearized spectrum studied in this section. The cubic vertices (2.3.27) will

enter the derivation of the K4 worldsheet action in Sec. 2.5.

2.3.2.2 Background gauge

For the effective-action calculation in Sec. 2.5, it is convenient to use instead the background

gauge [32–34]

∂µδAµ + (iδϕ˜︁ϕ∗ − iδϕ∗˜︁ϕ) = 0 , (2.3.29)

the standard choice in fluctuation analyses around solitonic backgrounds. It corresponds to

the Rξ gauge at ξ = 1, with gauge-fixing term

Lgf = −1

2

(︂
∂µδA

µ + i δϕ ˜︁ϕ∗ − i δϕ∗ ˜︁ϕ)︂2 , (2.3.30)
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whose virtue is to cancel the derivative mixing between the gauge and scalar fluctuations,

rendering the kinetic terms diagonal. Unlike the unitary gauge, this condition leaves a

residual gauge freedom, compensated by Faddeev–Popov ghosts with Lagrangian

Lgh = c
(︂
−□− 2|˜︁ϕ|2 − δϕ ˜︁ϕ∗ − δϕ∗ ˜︁ϕ)︂ c , (2.3.31)

where c, c are the ghost and anti-ghost fields. Including the gauge-fixing and ghost terms,

the action expanded about the ANO background reads

SB = −Tn
∫︂
d2σ + S

(2)
B + S

(3)
U + S

(4)
U + Sghost , (2.3.32)

with

S
(2)
B =

1

e2

∫︂
d4x

1

2

[︂
(δΨ(D))†DδΨ(D) + δAα

(︂
□ + 2|˜︁ϕ|2 )︂ δAα]︂ , (2.3.33)

and

Sghost =
1

e2

∫︂
d4x

[︂
−c(□+ 2|˜︁ϕ|2)c+ (︁− cδϕ ˜︁ϕ∗c+ h.c.

)︁]︂
. (2.3.34)

The two gauge choices lead to closely related quadratic actions, S(2)
U and S(2)

B , and must give

the same gauge-invariant physics. In particular, the dilaton-channel operator D is the same

in the two descriptions, and the worldsheet gauge-field components are governed by the same

transverse operator −∇2
i +2|˜︁ϕ|2. These operators, however, should not be identified directly

with the physical spectrum before gauge redundancy is removed. In the unitary-gauge de-

scription, the physical subspace is selected directly by imposing the gauge constraint (2.3.16)

in the dilaton channel and the transversality condition (2.3.25) in the axion channel. In the

background-gauge description, the corresponding projection is implemented by keeping the

Faddeev–Popov ghosts and using BRST cohomology. For both this section and the next, we

use the unitary gauge, where the physical constraints are imposed directly. We will return

to the background gauge in Sec. 2.5, where it is more convenient for deriving the effective

action.
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2.3.3 Dilaton channel

To determine the full fluctuation spectrum, we must solve the eigenvalue problems in both

the dilaton and axion channels. We begin with the dilaton channel. The physical modes

are solutions of the transverse eigenvalue problem for D⊥, subject to the unitary-gauge

constraint (2.3.16). We first reduce the four-dimensional linearized equation to a transverse

eigenvalue problem, then decompose the modes into transverse-spin sectors, and finally use

the resulting eigenfunctions to expand the four-dimensional fluctuations in worldsheet fields.

2.3.3.1 Transverse reduction and spin decomposition

Because the ANO background is independent of (t, z), we exploit the worldsheet translational

invariance to separate off the longitudinal dependence,11

δϕ = eiMt δϕ⊥(r, θ) , (2.3.35a)

δϕ∗ = e−iMt δϕ∗
⊥(r, θ) , (2.3.35b)

δAi = eiMt δAi,⊥(r, θ) , (2.3.35c)

where the subscript ⊥ denotes dependence on the transverse coordinates alone. We set the

longitudinal momentum to pz = 0; the general solution is recovered by a Lorentz boost along

z. Inserting (2.3.35) into the linearized equations (2.3.22) gives the transverse eigenvalue

problem

D⊥

⎛⎜⎜⎜⎜⎜⎜⎝
δϕ⊥

δϕ∗
⊥

δA+,⊥

δA−,⊥

⎞⎟⎟⎟⎟⎟⎟⎠ =M2

⎛⎜⎜⎜⎜⎜⎜⎝
δϕ⊥

δϕ∗
⊥

δA+,⊥

δA−,⊥

⎞⎟⎟⎟⎟⎟⎟⎠ , (2.3.36)

where D⊥ is the transverse part of D, obtained by stripping off the worldsheet Laplacian,

D = −∇2
α I4×4 −D⊥ , (2.3.37)

11 Since D commutes with ∂t, its eigenmodes can be chosen with definite frequency. Only the coupled
four-component block must share a common eigenvalue M2, and hence a common factor eiMt; the ansatz
below makes this explicit.
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and given explicitly by

D⊥ =

⎛⎜⎜⎜⎜⎜⎜⎝
K (β − 1)˜︁ϕ2 −2iD−˜︁ϕ −2iD+

˜︁ϕ
(β − 1)˜︁ϕ∗2 K∗ 2iD−˜︁ϕ∗ 2iD+

˜︁ϕ∗

2iD+
˜︁ϕ∗ −2iD+

˜︁ϕ −∇2
i + 2|˜︁ϕ|2 0

2iD−˜︁ϕ∗ −2iD−˜︁ϕ 0 −∇2
i + 2|˜︁ϕ|2

⎞⎟⎟⎟⎟⎟⎟⎠ , (2.3.38)

with all spatial indices lowered, and

K = −∇2
i − 2i ˜︁Ai∇i + ˜︁A2

i + β (2|˜︁ϕ|2 − 1) + |˜︁ϕ|2 . (2.3.39)

We next exploit the transverse rotational symmetry SO(2)⊥, organizing the fields into

eigenmodes of angular momentum m ∈ Z,12

δϕ⊥ =
∑︂
m∈Z

sm(r) e
i(n+m)θ , δϕ∗

⊥ =
∑︂
m∈Z

s∗−m(r) e
−i(n−m)θ , (2.3.40a)

δA+,⊥ =
∑︂
m∈Z

igm(r) e
i(m−1)θ , δA−,⊥ = −

∑︂
m∈Z

ig∗−m(r) e
i(m+1)θ . (2.3.40b)

The factors of ±i in the expansions of δA± are chosen so that the reduced operator is

manifestly real, while the pairing of sm with s∗−m and of gm with g∗−m makes the complex-

conjugation relations among the fields manifest at the level of mode functions; both features

streamline the numerical treatment. Inserting (2.3.40) into (2.3.36) decouples the spins,

reducing D⊥ in each spin-m sector to a real radial operator R(m),

R(m)

⎛⎜⎜⎜⎜⎜⎜⎝
sm

s∗−m

gm

g∗−m

⎞⎟⎟⎟⎟⎟⎟⎠ =M2

⎛⎜⎜⎜⎜⎜⎜⎝
sm

s∗−m

gm

g∗−m

⎞⎟⎟⎟⎟⎟⎟⎠ , (2.3.41)

with

R(m) =

⎛⎜⎜⎜⎜⎜⎜⎝
D+ V M1 M2

V D− M2 M1

M1 M2 C+ 0

M2 M1 0 C−

⎞⎟⎟⎟⎟⎟⎟⎠ , (2.3.42)

12 The phase factors ei(n±m)θ encode the effect of the background winding, ensuring that each term carries
definite transverse spin m.
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and entries

D± = −∇2
r +

(n(α + 1)±m)2

r2
+ f 2 + β(2f 2 − 1) , (2.3.43a)

C± = −∇2
r +

(−1±m)2

r2
+ 2f 2 , V = (β − 1) f 2 , (2.3.43b)

M1 =
√
2

(︃
df

dr
− nf

r
(1 + α)

)︃
, M2 = −

√
2

(︃
df

dr
+
nf

r
(1 + α)

)︃
, (2.3.43c)

where ∇2
r ≡ ∂2r +

1
r
∂r. Together with the angular factors in (2.3.40), the radial eigenfunctions

of (2.3.41) furnish a basis of solutions χ(D)
m,Nm

of the transverse eigenvalue equation

D⊥χ
(D)
m,Nm

=
(︂
M

(D)
m,Nm

)︂2
χ
(D)
m,Nm

, (2.3.44)

where m labels the spin, Nm the radial level, and the superscript D the dilaton channel; we

suppress these labels when no confusion arises. Not all of these solutions are physical: the

gauge condition (2.3.16) must still be imposed, to which we turn next.

2.3.3.2 Spin sectors, transverse parity, and the gauge constraint

The transverse-parity relation CRy R(α)CR
−1
y = R(−α) ties the spin-m and spin-(−m)

sectors together. At the level of the radial operator,

R(−m) = C R(m) C−1 , C ≡

⎛⎜⎜⎜⎜⎜⎜⎝
0 1 0 0

1 0 0 0

0 0 0 1

0 0 1 0

⎞⎟⎟⎟⎟⎟⎟⎠ , (2.3.45)

so that if ζ is an eigenmode of R(m) with eigenvalue M2, then Cζ is an eigenmode of R(−m)

with the same eigenvalue. It therefore suffices to takem ≥ 0, the spin-(−m) partner following

from C; this is the radial counterpart of the degenerate O(2)⊥ doublets. Since R(m) is real, we

may take its eigenvectors real,13 attaching conjugate coefficients to build complex solutions.

The spin-0 sector is special: there R(0) commutes with transverse parity,

[R(0), C] = 0 , (2.3.46)

13 The gauge condition is likewise real and transforms compatibly under C, so this restriction is consistent
with the construction of the physical mode basis.
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so it decomposes into the two eigenspaces of C, labeled by P⊥ = ±. For a complex mode

(s0, s
∗
0, g0, g

∗
0)
T these are

P⊥ = + :

⎛⎜⎜⎜⎜⎜⎜⎝
Re s0

Re s0

Re g0

Re g0

⎞⎟⎟⎟⎟⎟⎟⎠ , P⊥ = − :

⎛⎜⎜⎜⎜⎜⎜⎝
Im s0

−Im s0

Im g0

−Im g0

⎞⎟⎟⎟⎟⎟⎟⎠ , (2.3.47)

and the four-component eigenvalue problem splits into two two-component ones. In the even

sector, ⎛⎝ D+ + V M1 +M2

M1 +M2 C+

⎞⎠⎛⎝Re s0

Re g0

⎞⎠ =M2

⎛⎝Re s0

Re g0

⎞⎠ , (2.3.48)

and in the odd sector,⎛⎝ D+ − V M1 −M2

M1 −M2 C+

⎞⎠⎛⎝Im s0

Im g0

⎞⎠ =M2

⎛⎝Im s0

Im g0

⎞⎠ . (2.3.49)

We now impose the gauge condition (2.3.16). In the spin-m sector it becomes the radial

constraint

sm − s∗−m − (1−m+ r∂r)gm√
2 rf

+
(m+ 1 + r∂r)g

∗
−m√

2 rf
= 0 . (2.3.50)

For m ̸= 0, this single relation removes one of the four components. It is convenient to

pass to the CRy-covariant combinations s(±)
m = 1

2
(sm ± s∗−m) and g

(±)
m = 1

2
(gm ± g∗−m), in

which (2.3.50) determines g(+)
m algebraically; eliminating it leaves the physical spectrum

governed by a three-component eigenvalue problem for (s(+)
m , s

(−)
m , g

(−)
m ). The covariant basis

can be chosen to avoid inverse powers of r near the origin and improve numerical stability.

For m = 0, the effect of the gauge condition depends on the parity. In the even (P⊥ = +)

sector it is satisfied automatically, so every solution of (2.3.48) is physical. In the odd

(P⊥ = −) sector it further restricts the solutions of (2.3.49), reducing that two-component

problem to a single radial equation.

In summary, the physical dilaton spectrum is obtained by solving the three-component

problem described above for m > 0, the even spin-0 problem (2.3.48), and the constrained
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odd spin-0 problem. The gauge condition removes exactly one unphysical degree of freedom

from each spin sector, leaving the physical dilaton modes.

2.3.3.3 Worldsheet fields

The constrained eigenfunctions define the physical transverse profiles of the dilaton-channel

worldsheet particles. We denote these profiles by χ(D)
m,Nm

(r, θ), with worldsheet massesM (D)
m,Nm

.

The corresponding four-dimensional fluctuation can be expanded in this basis.

Since the radial operators are real, their eigenfunctions may be taken real, and the com-

plex structure is carried entirely by the worldsheet coefficients. For m ̸= 0, the spin-±m

sectors are related by complex conjugation and retain complex coefficients, while for m = 0

the even and odd subsectors are parametrized by real coefficients, with an explicit factor of

i extracted in the odd sector. For the effective-action analysis it is most useful to write this

expansion schematically in terms of the associated worldsheet fields,⎛⎜⎜⎜⎜⎜⎜⎝
δϕ

δϕ∗

δA+

δA−

⎞⎟⎟⎟⎟⎟⎟⎠ = χ
(D)
1,0 Y

+(σ) + χ
(D)
−1,0 Y

−(σ) +
∑︂
N0,+

χ
(D)
0,+,N0,+

φ+
N0,+

(σ) + i
∑︂
N0,−

χ
(D)
0,−,N0,−

φ−
N0,−

(σ)

+
∑︂
N2

(︂
χ
(D)
2,N2

B++
N2

(σ) + χ
(D)
−2,N2

B−−
N2

(σ)
)︂
+ · · · , (2.3.51)

where Y ± and B±±
N2

are complex-conjugate pairs of worldsheet fields, while φ+
N0,+

and φ−
N0,−

are real. Here Y ± are the spin-±1 translational zero modes and φ+ the worldsheet dilatons,

whose spectra are analyzed in Sec. 2.4.

2.3.4 Axion channel

The physical axion modes are the worldsheet gauge components δAα obeying the wave

equation (2.3.26) and the transversality constraint (2.3.25). We first solve the wave equation

and then impose the constraint on the polarization. As in the dilaton channel we separate

the worldsheet and transverse dependence and expand the transverse profile in angular-

29



momentum eigenmodes,

χ
(A)
m,Nm

(r, θ) = χ
(A)
m,Nm

(r) eimθ , (2.3.52)

where, with a slight abuse of notation, χ(A)
m,Nm

denotes both the transverse profile and its

radial part. The profile satisfies(︂
−∇2

i + 2|˜︁ϕ|2)︂χ(A)
m,Nm

(r, θ) =
(︂
M

(A)
m,Nm

)︂2
χ
(A)
m,Nm

(r, θ) , (2.3.53)

which reduces to the radial equation(︃
−∇2

r +
m2

r2
+ 2f 2

)︃
χ
(A)
m,Nm

(r) =
(︂
M

(A)
m,Nm

)︂2
χ
(A)
m,Nm

(r) . (2.3.54)

The full axion fluctuation is then expanded as

δAα =
∑︂
m∈Z

∑︂∫︂
Nm

∫︂ ∞

−∞

˜︂dkz [︂ϵα(k) am,Nm(k)χ
(A)
m,Nm

(r, θ)e−ik·σ + h.c.
]︂
, (2.3.55)

with worldsheet momentum kα =
(︁√︂

(M
(A)
m,Nm

)2 + k2z , kz
)︁

and measure ˜︂dkz ≡ dkz/(2π
√
2k0).

The transversality constraint (2.3.25) leaves a single physical worldsheet polarization, nor-

malized as

ϵα(k) =
1

M
(A)
m,Nm

ϵαβk
β , ϵ∗α(k)ϵ

α(k) = −1 . (2.3.56)

We use ϵ01 = 1 and ϵ01 = −1 on the flat worldsheet.

Having constructed the transverse profiles in both channels, we close this section

by recording two properties of these bases that underlie the mode expansions (2.3.51)

and (2.3.55) and that we use repeatedly in the sequel. The eigenfunctions of (2.3.9)

and (2.3.10) are orthonormal in the transverse inner product,∫︂ 2π

0

dθ

∫︂ ∞

0

dr r χ†
m,Nm

(r, θ)χn,Nn(r, θ) = δm,n δNm,Nn , (2.3.57)

For the full eigenbasis before imposing the physical constraints, completeness on the trans-

verse plane reads ∑︂
m

∑︂∫︂
Nm

χm,Nm(r
′, θ′)χ†

m,Nm
(r, θ) =

1

r
δ(r − r′) δ(θ − θ′) I , (2.3.58)
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where the sum runs over both bound and continuum states, and I is the identity on the

appropriate fluctuation space: I4×4 for the dilaton profiles χ(D)
m,Nm

and 1 for the axion profiles

χ
(A)
m,Nm

. These relations normalize the translational zero modes of the string in Sec. 2.4 and

supply the summation rule used to integrate out the massive fluctuations in Sec. 2.5.

2.4 Fluctuation Spectrum

In this section, we analyze the fluctuation spectrum of the ANO string, classifying the

modes by their quantum numbers and presenting the corresponding numerical results. The

spectrum depends on both the winding number n and the mass ratio β. As discussed in

Sec. 2.2.2, dimensionful quantities can be restored by dimensional analysis, and all mass-

squared eigenvalues M2 in the eigenvalue equations (2.3.9) and (2.3.10) are expressed in

units of (ev)2.

For stable strings, there are three types of fluctuations: (i) zero modes, which lie in the

kernel of the second-order transverse fluctuation operator in (2.3.38); (ii) discrete bound

states, which are normalizable eigenfunctions describing internal excitations of the string;

and (iii) continuum scattering states, which are non-normalizable eigenfunctions. In addition,

for strings in the type-II regime, β > 1, the n-string configuration with n > 1 is unstable

and tends to decay into n fundamental strings. This instability appears as tachyonic modes

with negative energy in the fluctuation spectrum.

The main features of the spectrum can be summarized as follows. Every n-string carries

two universal zero modes, the transverse translational Goldstone bosons of spin ±1. Above

these, the low-lying spectrum is organized into two light worldsheet scalars – a 0++ dilaton

and a 0−− axion – together with a tower of higher-spin bound states. The axion is always

present as a bound state, whereas the dilaton and the higher-spin states are bound only in

part of the (n, β) plane. At the BPS point β = 1 the dilaton and axion become degenerate,

reflecting the underlying N = 1 supersymmetry, and the spins 1, . . . , n collapse to a set of

2n zero modes–the moduli of the multi-string configuration. Moving into the type-II regime
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β > 1 lifts these moduli to negative mass squared; the resulting tachyons signal the decay of

the n-string, and the leading instability is the spin-two doublet 2+. All of these orderings,

in the spin m, the winding n, and the coupling β, follow from the centrifugal structure of

the radial fluctuation operators.

We begin in section 2.4.1 by classifying the modes according to their quantum num-

bers. In section 2.4.2 we discuss the zero modes, which arise only in the dilaton channel.

Section 2.4.3 then treats the two light scalars, the worldsheet dilaton and axion, and sec-

tion 2.4.4 the higher-spin tower and the type-II instability. The figures below display the

numerical spectra.

2.4.1 Mode Classification

Given the unbroken symmetries O(1, 1)∥ × O(2)⊥ discussed in Sec. 2.3.1, the fluctuation

spectrum is classified by their quantum numbers. We begin by classifying the modes under

the transverse symmetry O(2)⊥. They are labeled by the SO(2)⊥ spin m: for |m| ̸= 0,

the states with spins ±m are exchanged by the transverse reflection and together form

degenerate O(2)⊥ doublets, while for m = 0 the modes are O(2)⊥ singlets labeled by the

reflection eigenvalue P⊥. In the longitudinal direction, the modes in the rest frame can be

further classified by the worldsheet parity P∥. Thus, the m = 0 modes are labeled by 0P⊥P∥ ,

whereas for |m| ̸= 0 the doublets may be labeled either by mP∥ in the spin-diagonal basis or

by |m|P⊥P∥ in the parity-diagonal basis. In what follows, for the doublets we will focus on the

m > 0 modes and denote the corresponding doublets simply by mP∥ , with the understanding

that the partner state with spin −m is obtained by acting with P⊥.

This structure is already visible in the mode expansion and radial eigenvalue equations

of the previous section. There, the fluctuations were first decomposed into sectors of definite

spin m in the dilaton and axion channels, see (2.3.41) and (2.3.54). In the m = 0 sector, the

dilaton channel further splits into two decoupled radial eigenvalue equations, (2.3.48) and

(2.3.49), corresponding to the 0++ and 0−+ sectors, respectively, while the physical axion

equation (2.3.54) lies in the 0−− sector. The decomposition of the radial equations therefore
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directly matches the quantum number classification of the modes.

For each fixed set of quantum numbers, the fluctuation eigenequations admit scattering

states and, in some channels, a discrete tower of bound states labeled by an excitation index

Nm. Their corresponding eigenvalues are interpreted as the worldsheet mass squared of these

modes, or equivalently as the eigenvalues of the quadratic Casimir of the worldsheet Poincare

group ISO(1, 1).

2.4.2 Zero Modes

For all strings, there exist two universal zero-eigenvalue modes associated with the sponta-

neous breaking of translational symmetry in the two transverse directions. These field con-

figurations correspond to gauge-fixed translations of the classical ANO string background

(2.2.11), defined by the covariant derivative with the background gauge field [32],

δkϕ = ˜︁Dk
˜︁ϕ = ∂k˜︁ϕ+ i ˜︁Ak˜︁ϕ , δkAj = ˜︁Fkj , (2.4.1)

where k labels the two transverse directions. Since they involve only variations of the scalar

field δϕ and the transverse components of the gauge field δAi, these modes appear in the

dilaton channel. The translational zero modes take the form

χ
(D)
−1,0 =

1
√
cχ

⎛⎜⎜⎜⎜⎜⎜⎝
˜︁D+
˜︁ϕ˜︁D+
˜︁ϕ∗

F++

F+−

⎞⎟⎟⎟⎟⎟⎟⎠ =
1

√
cχ

⎛⎜⎜⎜⎜⎜⎜⎝

eiθ(n−1)(rf ′+nf(α+1))√
2r

e−iθ(n+1)(rf ′−nf(α+1))√
2r

0

inα′

r

⎞⎟⎟⎟⎟⎟⎟⎠ (2.4.2)

χ
(D)
1,0 =

1
√
cχ

⎛⎜⎜⎜⎜⎜⎜⎝
˜︁D−˜︁ϕ˜︁D−˜︁ϕ∗

F−+

F−−

⎞⎟⎟⎟⎟⎟⎟⎠ =
1

√
cχ

⎛⎜⎜⎜⎜⎜⎜⎝

eiθ(n+1)(rf ′−nf(α+1))√
2r

e−iθ(n−1)(rf ′+nf(α+1))√
2r

− inα′

r

0

⎞⎟⎟⎟⎟⎟⎟⎠ (2.4.3)

These modes are normalizable, and the normalization constant cχ, chosen to satisfy

Eq. (2.3.57), is given by

cχ = 2π

∫︂ ∞

0

dr
n2α′2 + n2(α + 1)2f 2 + r2f ′2

r
. (2.4.4)
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Using the equations of motion for the vortex background (2.2.11), one can verify that these

modes lie in the kernel of the fluctuation operator (2.3.38):

D⊥χ
(D)
±1,0 = 0 (2.4.5)

and trivially satisfy the gauge constraints (2.3.16).

These two zero modes correspond precisely to the universal Nambu–Goldstone bosons

associated with the spontaneous breaking of transverse translational symmetry. They carry

spins ±1 and have P∥ = +. In the notation introduced above, they form a massless doublet,

denoted simply by 1+.

At the BPS limit, β = 1, the vortex string background possesses a 2n-dimensional mod-

uli space [35, 36]. These moduli are identified as the positions of the n vortices in the

spatial xy−plane. The associated moduli manifest as zero modes in the fluctuation spec-

trum, giving rise to normalizable modes with spins ±1,±2, . . . ,±n, all in the dilaton channel.

These modes form the massless doublets 1+ , 2+ , . . . , n+, which describe internal deforma-

tions of the multi-string configuration within the moduli space. Away from the BPS point,

these modes with spin |m| > 1 are no longer massless. In the type-II regime with β > 1, they

acquire a negative mass squared and thus become tachyonic, signaling that the multi-vortex

configuration with n > 1 is unstable. In contrast, in the type-I regime with β < 1, these

modes remain stable and can be either bound or scattering states, depending on the value

of β. We will return to these details below. In the following, unless stated otherwise, zero

modes refer to the universal spin-±1 translational modes of the string.

2.4.3 The Light Scalars: Worldsheet Dilaton and Axion

In addition to the zero modes, the second-order string fluctuation operator admits a massive

spectrum consisting of continuum scattering states and, in some sectors, discrete bound

states. Its detailed structure depends sensitively on the mass-squared ratio β and the winding

number n. In the dilaton channel, the continuum starts at M2 = min{m2
H , m

2
V }, while in the

axion channel it starts at M2 = m2
V . Here m2

H and m2
V are given in (2.2.3); in units of e2v2,
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they are 2β and 2, respectively. These thresholds are the same in every spin sector, a fact

used repeatedly in the analysis below: at large r the profile approaches the Higgs vacuum,

f → 1, so the axion equation (2.3.54) reduces to −∇2
r + 2 and the coupled dilaton system

to a diagonal form with the same asymptotic potential, fixing the thresholds quoted above

independently of the spin. As discussed below, massive discrete bound states are always

present in the axion channel, whereas in the dilaton channel their existence depends on the

values of β and n.

We begin with the two lightest scalars – the 0++ dilaton and the 0−− axion, presenting the

two channels side by side, since it is their comparison that carries the physics; the higher-spin

tower follows in Sec. 2.4.4.

The spin-0 fluctuations decompose into three sectors,14

0++ , 0−+ , 0−− . (2.4.6)

The first two arise from the dilaton channel and are governed by Eq. (2.3.48) and the gauge-

constrained odd-sector equation, respectively, while the last arises from the axion channel

and is governed by Eq. (2.3.54).

The first two arise from the dilaton channel and the last from the axion channel, and we

take them in turn. The 0++ sector carries a continuum of scattering states with threshold

at M2 = min{2, 2β} and, throughout the type-I regime and for sufficiently small β in the

type-II regime, at least one normalizable bound state—the worldsheet dilaton. The range

of β over which this bound state exists widens with the winding n; within it, the mass of

the lightest state increases with β and decreases with n, while larger n or smaller β can

bind additional levels. Beyond this range the sector is purely continuous. The 0−+ sector,

by contrast, supports no bound states at all: our numerical scan over β ∈ [0.1, 10] and

n = 1, . . . , 5 finds only continuum scattering states.

The 0−− sector belongs to the axion channel, whose physical modes all carry P∥ = −;

the spin-zero states are odd under both P⊥ and P∥ and are the worldsheet axions. Here

14 Since only the axion channel carries P∥ = −, and P⊥ acts trivially in the axion channel, there is no 0+−

sector.
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the continuum sets in at M2 = 2, and there is always at least one bound state below it, as

expected for an attractive two-dimensional potential well [37]. As in the 0++ sector, this

lightest axion becomes lighter as n increases or β decreases. The behaviour of both light

scalars with β for n = 1 is displayed in Fig. 2.2.

It is also instructive to compare the lightest bound states in the 0++ dilaton sector and

the 0−− axion sector. We find that the lightest dilaton is lighter than the lightest axion

in the type-I regime, while in the type-II regime the ordering is reversed and the lightest

axion becomes lighter. At the BPS point β = 1, the two masses coincide. This is consistent

with the fact that, at the BPS point, the Abelian Higgs model admits an embedding into an

N = 1 supersymmetric theory, suggesting a natural relation between these two worldsheet

excitations. This comparison of the two masses is shown in Fig. 2.2.

We present numerical results for the lightest bound states in the 0++ dilaton sector and

the 0−− axion sector. For n = 1 and representative values of β, we numerically solve the

corresponding eigenvalue equations, Eqs. (2.3.48) and (2.3.54), and extract the lowest mass-

squared eigenvalues. The spectra plotted below show how the lightest axion and dilaton

masses vary with β, including the change in their ordering across the type-I and type-II

regimes.

2.4.4 Higher-Spin Modes and the Type-II Instability

In the following discussion, we restrict to the representative with m > 0, with the under-

standing that the partner state with spin −m is generated by P⊥; equivalently, we describe

the corresponding degenerate doublets. We now turn to the sectors with m ≥ 1. In the dila-

ton channel, these modes have P∥ = + and are denoted by m+, while in the axion channel

they have P∥ = − and are denoted by m−.

As in the spin-0 sectors, the spectrum contains a continuum of scattering states, with

threshold at M2 = min{2, 2β} in the dilaton channel and M2 = 2 in the axion channel.

In addition to the zero modes discussed in Sec. 2.4.2, there may also exist massive bound

states, whose detailed structure depends on β and n.
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Figure 2.2: Mass squared of the lightest dilaton 0++ and axion 0−− as a function of β for the

fundamental n = 1 string. The pink shading marks the region above the axion bound-state

threshold m2
V , while the blue and pink shading together mark the region above the dilaton

bound-state threshold min{m2
H ,m

2
V }. The green dashed line marks the BPS point β = 1.

The spins in the window 2 ≤ m ≤ n play a distinguished role, and the dilaton modes

m+ there are the most interesting feature of the higher-spin spectrum. Their lowest state

behaves qualitatively differently in the three regimes. At the BPS point β = 1 it is massless—

a modulus of the internal deformations of the multi-string configuration, part of the enlarged

moduli space of Sec. 2.4.2. In the type-II regime β > 1 it acquires negative mass squared

and becomes tachyonic, signalling the instability of the cylindrically symmetric n ≥ 2 vortex

under the repulsive inter-string force. In the type-I regime β < 1 it acquires positive mass

and is a stable internal excitation, reflecting the attractive force that binds the constituent

strings. The spin-±1 sector is exceptional: it always contains the universal translational zero

modes of Sec. 2.4.2, which remain massless for every β.

Because raising the spin can only raise the mass squared, the leading instability of the
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type-II n-string is the lowest member of this window, the spin-two doublet 2+: the tachyons

are orderedM2
2 ≤M2

3 ≤ · · · ≤M2
n < 0 for β > 1, proved for n = 2 and confirmed numerically

for n ≥ 3.

Outside this window, for the dilaton modes m+ and the axion modes m− with m > n,

the present numerical scan finds no bound states. The pattern across the whole tower is

uniform and traces back to the centrifugal ordering: bound states are favoured, and lighter,

at larger n, smaller β, and smaller m, so that the number of levels below threshold falls as

the spin is raised and vanishes beyond m = n.

We close with the organizing principle behind these trends. The spin m enters the radial

fluctuation operators only through non-negative centrifugal terms, so raising the spin can

only raise the mass squared, while the winding n and coupling β enter only through the

background profile. The orderings in m, n and β—the axion tower rising with |m|, the light

dilaton and axion crossing at the BPS point, the moduli at spins 1, . . . , n, and the spin-two

tachyon that controls the type-II instability—are all consequences of this structure.

2.5 Effective String Action: O(K4) Curvature Correction

In this section we derive the leading higher-curvature corrections to the Nambu–Goto action

for the ANO string by integrating out the massive fluctuation modes of the vortex identified

in the previous sections. These corrections appear at weight four in the effective string

action, with coefficients determined by the massive worldsheet spectrum and by the cubic

couplings of its modes to two zero modes.

2.5.1 Overview

As reviewed in Sec. 2.1, the low-energy dynamics of a long string is described by the Gold-

stones X i. In the Abelian Higgs model, these modes are accompanied by a tower of massive

modes in the fluctuation spectrum of the vortex. At energies much lower than the massive

scale, their leading effect can be viewed as tree-level exchange between pairs of translational
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zero modes, 15 shown in Fig. 2.3. In the low-energy expansion, this exchange reduces to the

leading O(K4) corrections to the Nambu–Goto action. This section makes this exchange

picture explicit.

Q Q

Xi

X j

Xk

Xl

massive

modes

1

M2

Figure 2.3: Tree-level exchange of a massive worldsheet mode between two pairs of transla-

tional zero modes. Integrating out the exchanged mode gives the leading O(K4) contribution

to the effective string action. At this order, only the 0++, 0−−, and 2+ sectors contribute.

Worldsheet diffeomorphism invariance and spacetime Poincare symmetry strongly restrict

which massive sectors can contribute at this order. Only three sectors can appear in the cubic

vertices relevant for tree-level exchange: the scalar 0++ sector, the pseudoscalar 0−− sector,

and the spin-two 2+ sector. Denoting the corresponding worldsheet fields by φ, a, and Bij,

their leading couplings to the translational Goldstones take the geometric form [38, 39]

16

Sφ =

∫︂
d2˜︁σ√−h

(︃
1

2
(˜︁∂αφ)2 − 1

2
m2
φφ

2 +Qφ φR

)︃
, (2.5.1)

Sa =

∫︂
d2˜︁σ√−h

(︃
1

2
(˜︁∂αa)2 − 1

2
m2
aa

2 +Qaϵ
βγϵij aK

i
αβK

α
γ
j

)︃
, (2.5.2)

SB =

∫︂
d2˜︁σ√−h

(︃
1

2
(˜︁∂αBij)

2 − 1

2
m2
BB

2
ij +QBBij(K

i
αβK

αβj − 1

2
δijR)

)︃
. (2.5.3)

Here Qφ, Qa, and QB are the corresponding cubic couplings.

15 At low energies the Goldstones Xi are naturally organized into geometric quantities of the worldsheet.
Since the first nontrivial corrections to the Nambu–Goto action occur at weight four, the relevant massive-
mode sources are quadratic in the extrinsic curvature, schematically O(K2). The leading terms of these
sources correspond microscopically to cubic vertices involving one massive mode and two zero modes.

16 Throughout this section, ˜︁σ and ˜︁∂ denote the dimensionful worldsheet coordinates and derivatives,
respectively, in order to distinguish them from the dimensionless ones.
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Integrating out these massive modes at tree level produces the leading O(K4) correction

in the effective string action. 17 The resulting terms can be matched to the effective string

action in (2.1.8) and (2.1.11). We repeat them here for convenience:

Seff =

∫︂
d2σ

√
−h
[︂
−T + cR2R2 + cK4Ki

αβK
αβ
j Ki

γδK
γδ
j + · · ·

]︂
. (2.5.4)

For a single mode in each sector, the contributions are

cφR2 =
Q2
φ

2m2
φ

, caR2 =− Q2
a

m2
a

, cBR2 = − Q2
B

4m2
B

, (2.5.5)

caK4 =
Q2
a

m2
a

, cBK4 =
Q2
B

2m2
B

. (2.5.6)

The full coefficients cR2 and cK4 are obtained by summing over all modes in these sectors,

including both discrete and scattering states.

In practice, we will not evaluate the continuum contribution mode by mode. Instead, in

each symmetry sector the cubic vertex defines a fixed source profile. Using completeness,

the full exchange contribution can be rewritten as a matrix element of a power of the inverse

transverse fluctuation operator. This is the method used below to obtain the final O(K4)

coefficients cR2 and cK4 .

To extract these couplings from the Abelian Higgs action, we expand the curvature inter-

actions to leading order in static gauge and introduce the canonically normalized Goldstones

Y i ≡
√
T X i , (2.5.7)

the worldsheet action relevant at this order takes the form

Sws ⊃
∫︂
d2˜︁σ [︃−T +

1

2
(˜︁∂αY i)2 + Lφ + La + LB

]︃
, (2.5.8)

17 For a massive field φ coupled linearly as QφφJφ, solving its equation of motion and substituting back

gives Leff = 1
2Q

2
φJφ(∂

2 +m2
φ)

−1Jφ. At energies well below mφ, this reduces to Leff =
Q2

φ

2m2
φ
J2
φ +O(∂2/m4

φ).
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with

Lφ =
1

2
(˜︁∂αφ)2 − 1

2
m2
φφ

2 +
Qφ

T
φ ˜︁∂α˜︁∂βY i ˜︁∂α˜︁∂βY i , (2.5.9)

La =
1

2
(˜︁∂αa)2 − 1

2
m2
aa

2 +
Qa

T
a ϵijϵαβ˜︁∂α˜︁∂γY i ˜︁∂γ ˜︁∂βY j , (2.5.10)

LB =
1

2
(˜︁∂αBij)

2 − 1

2
m2
BB

2
ij +

QB

T
Bij

(︃˜︁∂α˜︁∂βY i ˜︁∂α˜︁∂βY j − 1

2
δij ˜︁∂α˜︁∂βY k ˜︁∂α˜︁∂βY k

)︃
. (2.5.11)

These expressions define the operator basis used below to match the cubic vertices obtained

from the Abelian Higgs model.

The rest of the section is organized as follows. In Sec. 2.5.2, we introduce the relevant

worldsheet fields, derive their action, and determine the couplings Qφ, Qa, and QB from the

Abelian Higgs model. We then use the completeness relation to obtain the Wilson coefficients

cR2 and cK4 for the ANO string in Sec. 2.5.3.

2.5.2 Worldsheet fields and action

We now identify the worldsheet fields and determine their cubic couplings from the Abelian

Higgs model. In this section, we work in the background gauge (2.3.29), which simplifies

the extraction of the tree-level K4 correction. This differs from the previous two sections,

where we used the unitary gauge to determine the physical spectrum. In the background

gauge, the physical and unphysical modes can instead be separated systematically using

BRST cohomology. However, we will not need this separation explicitly: by ghost number

conservation, the unphysical modes do not contribute to the tree-level exchange between

pairs of translational zero modes.

The transverse eigenmodes found in the previous sections provide a good basis for expand-

ing the four-dimensional fluctuations around the ANO vortex. 18 The coefficients of these

profiles become two-dimensional fields propagating along the string. As discussed above, we

just focus on the translational 1+ zero modes, the 0++ and 2+ modes in the dilaton channel,

and the 0−− modes in the axion channel.

18 The same transverse operators appear in the two gauge choices, while the physical projection is imple-
mented differently, as discussed above.

41



The relevant fluctuations in the two channels are expanded in transverse eigenmodes of

D⊥ and −∇2
i + 2|˜︁ϕ|2, respectively, as 19

⎛⎜⎜⎜⎜⎜⎜⎝
δϕ

δϕ∗

δA+

δA−

⎞⎟⎟⎟⎟⎟⎟⎠ = e

[︄
χ
(D)
1,0 Y

+(σ) + χ
(D)
−1,0 Y

−(σ) +
∑︂∫︂
N0

χ
(D)
0,N0

φN0(σ)

+
∑︂∫︂
N2

(︂
χ
(D)
2,N2

B++
N2

(σ) + χ
(D)
−2,N2

B−−
N2

(σ)
)︂]︄

+ · · · , (2.5.12)

δAα = e
∑︂∫︂
N0

χ
(A)
0,N0

(r, θ)
1

M
(A)
0,N0

ϵαβ∂
βaN0(σ) + · · · . (2.5.13)

20 The coefficients in these mode expansions realize the worldsheet fields introduced above

in the Abelian Higgs model. In the complex basis, the Goldstone and spin-2 fields satisfy

(Y ±)∗ = Y ∓ , (B±±
N2

)∗ = B∓∓
N2

. (2.5.14)

The sums run over all modes in the relevant massive sectors, while the ellipses denote modes

that will not be needed below.

We now insert the mode expansions (2.5.12) and (2.5.13) into the Abelian Higgs fluc-

tuation action (2.3.32). Keeping the quadratic terms and the cubic terms involving one

massive field and two translational zero modes, we obtain the worldsheet action relevant for

19 While this schematic form of δAα expansion mirrors the structure of the on-shell mode expansion, care
must be taken when using it to compute kinetic terms. In particular, substituting it directly into the kinetic
term leads to higher-derivative expressions that are ill-defined off-shell. A well-defined kinetic Hamiltonian
instead follows from the properly normalized mode expansion given in Eq. (2.3.55), which yields a canonical
Hamiltonian in the axion channel. Once the kinetic structure is fixed in this way, and using the on-shell
condition, the schematic expansion may then be used to extract higher-order interactions.

20 With this convention, the fields Y i, φN0 , aN0 , and Bij
N2

have canonical quadratic kinetic terms in the
reduced worldsheet action. The cubic vertices then carry one explicit power of e.
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the tree-level O(K4) correction: 21

∫︂
dt dz

[︄
1

2
(∂αY

i)2 +
∑︂∫︂
N0

[︄
1

2
(∂αφN0)

2 − 1

2
(M

(D)
0,N0

)2φ2
N0

+ e κφ,N0 φN0Y
+Y −

]︄

+
∑︂∫︂
N0

[︄
1

2
(∂αaN0)

2 − 1

2
(M

(A)
0,N0

)2a2N0
+ e κa,N0

1

M
(A)
0,N0

ϵijϵαβ ∂
βaN0 Y

i∂αY j

]︄

+
∑︂∫︂
N2

[︄
1

2
(∂αBN2,ij)

2 − 1

2
(M

(D)
2,N2

)2B2
N2,ij + e κB,N2

(︂
Y +Y +B−−

N2
+ Y −Y −B++

N2

)︂]︄
+ · · ·

]︄
.

(2.5.15)

The three sectors in (2.5.15) share the same general structure. In the transverse eigen-

mode basis, the quadratic worldsheet action is diagonal: the fields φN0 , aN0 , and BN2,ij

have canonical kinetic terms, with masses given by the corresponding transverse eigenvalues.

Each massive mode also couples cubically to a bilinear of translational zero modes. These

couplings are given by overlap integrals of the massive mode profiles with the corresponding

zero mode bilinear sources:

κφ,N0 = 2π

∫︂ ∞

0

dr r χ
(D)†
0,N0

(r) ζφXX(r) , (2.5.16)

κa,N0 = 2π

∫︂ ∞

0

dr r χ
(A)†
0,N0

(r) ζaXX(r) , (2.5.17)

κB,N2 = 2π

∫︂ ∞

0

dr r χ
(D)†
2,N2

(r)ζBXX(r) , (2.5.18)

Here ζφXX , ζaXX , and ζBXX are the effective radial profiles generated by bilinears of the

translational zero modes after summing over the relevant cubic interaction terms. Explicitly,

21 Here we continue to work in units with ˜︁v = 1. Dimensionful quantities can be restored in powers of ev;
for example, the physical masses are evM .
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22

ζφXX(r) =

⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

−f (3βr
2f ′2 + (β − 2)n2f 2(α + 1)2)

cχr2

−f (3βr
2f ′2 + (β − 2)n2f 2(α + 1)2)

cχr2√
2n (rf ′ [(α + 1)(rf ′ − 2f) + 2rf α′] + n2f 2(α + 1)3)

cχr3√
2n (rf ′ [(α + 1)(rf ′ − 2f) + 2rf α′] + n2f 2(α + 1)3)

cχr3

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠
, (2.5.19)

ζaXX(r) =
2n f ′f(α+ 1)

r cχ
, (2.5.20)

and

ζBXX =

⎛⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎜⎝

−βfψ2
1 − 2βfψ2ψ1 +

√
2(α + 1)nψ3ψ1

r
+

√
2ψ3ψ1

r
−
√
2ψ3 ψ

′
1 −

ψ1 ψ
′
3√

2

−2βfψ2ψ1 − βfψ2
2 +

√
2(α+ 1)nψ3ψ2

r
−

√
2ψ3ψ2

r
+
√
2ψ3 ψ

′
2 +

ψ2 ψ
′
3√

2

−2fψ3ψ2 − 2fψ3ψ1 +

√
2(α + 1)nψ2ψ1

r
+
ψ2 ψ

′
1√

2
− ψ1 ψ

′
2√

2√
2(α + 1)nψ2ψ1

r
− ψ2 ψ

′
1√

2
+
ψ1 ψ

′
2√

2

⎞⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎟⎠
,

(2.5.21)

with

ψ1 =
1

√
cχ

rf ′ − nf(α + 1)√
2 r

, ψ2 =
1

√
cχ

rf ′ + nf(α + 1)√
2 r

, ψ3 = − 1
√
cχ

nα′

r
. (2.5.22)

Although the units with ˜︁v = 1 used in the four-dimensional analysis are convenient, the

string tension T provides a more natural scale for the worldsheet action. We therefore restore

the dimensionful worldsheet coordinates below. To match the microscopic vertices in (2.5.15)

to the effective string couplings in (2.5.9)–(2.5.11), we restore the scale ev, integrate by parts,

and use the free equations of motion for the worldsheet fields. The resulting interactions are

then written in the same operator basis.

22 This provides a direct check of the selection rule. The angular integral enforces transverse spin
conservation, so Y +Y − can only couple to spin-zero massive modes. Within this sector, ζφXX is orthogonal
to the 0−+ profiles in (2.3.47), leaving only the 0++ modes.
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For each mode, the couplings are

Qφ =
2τ(β)

e
(︂
M

(D)
0 (β)

)︂4 κφ(β) , (2.5.23)

Qa =
2τ(β)

e
(︂
M

(A)
0 (β)

)︂3 κa(β) , T ≡ τ(β)v2 (2.5.24)

QB =
4τ(β)

e
(︂
M

(D)
2 (β)

)︂4 κB(β) . (2.5.25)

where the dependence on β has been made explicit.

The cubic couplings are well defined for bound states, since they are given by overlap

integrals of normalizable profiles. The numerical values of eQφ,0 for the lightest dilaton

mode are summarized in Table 2.2. For scattering states, however, the eigenfunctions are

not normalizable, so individual couplings are not well defined by the overlap formulas above.

2.5.3 Completeness and O(K4) Wilsonian coefficients

The contribution of each massive mode to cR2 and cK4 is fixed by its mass and coupling,

as reviewed above. Summing over all discrete and continuum dilaton, axion, and spin-two

modes then gives the following sum rules:

cR2 = cφR2 + caR2 + cBR2 =
∑︂∫︂
N0

Q2
φ,N0

2(evM
(D)
0,N0

)2
−
∑︂∫︂
N0

Q2
a,N0

(evM
(A)
0,N0

)2
−
∑︂∫︂
N2

Q2
B,N2

4(evM
(D)
2,N2

)2
, (2.5.26)

cK4 = caK4 + cBK4 =
∑︂∫︂
N0

Q2
a,N0

(evM
(A)
0,N0

)2
+
∑︂∫︂
N2

Q2
B,N2

2(evM
(D)
2,N2

)2
. (2.5.27)

However, the scattering modes are non-normalizable, so the corresponding couplings Q

are not individually well defined and their contributions to cR2 and cK4 cannot be evaluated

mode by mode. Importantly, the completeness relation allows us to perform the continuum

sum directly, bypassing this difficulty and obtaining the full contribution. Similar methods

have been used in braneworld effective theories [40]. We now explain how this works.

From (2.5.23)–(2.5.27), the tree-level contributions to cR2 and cK4 take the same spectral
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sum form in each sector,

∑︂∫︂
N

κ2N
M2s

N

, (2.5.28)

where the integer s and the coefficient κN depend on the sector. We retain the four-

component radial profiles and sources in the dilaton channel. The angular factors contain no

1/
√
2π, so (2.3.57) gives 2π

∫︁∞
0
dr r χ†

N(r)χN ′(r) = δNN ′ at fixed spin. No additional radial

rescaling is made. Thus, consistently with (2.5.16)–(2.5.18),

κN = 2π

∫︂ ∞

0

dr r χ†
N(r) ζ(r) . (2.5.29)

Here ζ(r) is the zero mode bilinear source and is independent of the excitation level N . For

the completeness calculation, χN(r) runs over the full background-gauge eigenbasis at fixed

spin of the Hermitian operator ˆ︁Ω,

ˆ︁ΩχN(r) =M2
NχN(r) . (2.5.30)

The operator ˆ︁Ω is channel dependent: ˆ︁Ω = R(m) in the dilaton channel (2.3.41), and ˆ︁Ω =

−∂2r + m2

r2
+ 2f 2 in the axion channel (2.3.54).

We rewrite the source as

ζ(r) = ˆ︁ΩsG(r) , (2.5.31)

where G(r) satisfies boundary conditions for which the boundary terms vanish. If zero modes

are present, the inverse is defined on their orthogonal complement, and the source must lie

in that subspace.

The overlap coefficient then becomes

κN = 2π

∫︂ ∞

0

dr r χ†
N(r)

ˆ︁ΩsG(r)

= 2π

∫︂ ∞

0

dr r
(︂ˆ︁ΩsχN(r)

)︂†
G(r)

= 2πM2s
N

∫︂ ∞

0

dr r χ†
N(r)G(r) , (2.5.32)
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where we used the self-adjointness of ˆ︁Ω, the vanishing of the boundary terms, and the

eigenvalue equation ˆ︁ΩsχN =M2s
N χN .

Substituting this result into the spectral sum 23 and using the completeness relation

∑︂∫︂
N

χN(r)χ
†
N(ρ) =

1

2πr
δ(r − ρ) I , (2.5.33)

where I is the identity in the fluctuation space of the corresponding channel: I4×4 in the

dilaton channel and 1 in the axion channel. The sum uses the full eigenbasis at fixed spin;

the source ζφXX has zero overlap with the odd spin-zero modes. We obtain

∑︂∫︂
N

κ2N
M2s

N

= 2π

∫︂ ∞

0

dr r G†(r)ζ(r) . (2.5.34)

To avoid solving a high-order differential equation in practice, we may instead factor the

operator by writing s = s1 + s2, where s1, s2 ∈ Z≥0, and solve

ˆ︁Ωs1G1 = ζ , ˆ︁Ωs2G2 = ζ . (2.5.35)

Then the spectral sum becomes

∑︂∫︂
N

κ2N
M2s

N

= 2π

∫︂ ∞

0

dr r G†
1(r)G2(r) , (2.5.36)

reducing the differential order involved in the computation.

To summarize, the full spectral sum is obtained by solving for G in (2.5.31), or equiva-

lently for G1 and G2 in (2.5.35), and using (2.5.34) or (2.5.36). These expressions include

both bound and continuum states without summing over the spectrum mode by mode. Alter-

natively, the continuum contribution can be isolated by subtracting the discrete bound-state

sum from the full result.

We now apply the procedure described above to the three relevant sectors. As discussed

23 For a real radial basis,
∫︁∞
0
dr r G†(r)χN (r) =

∫︁∞
0
dr r χ†

N (r)G(r).
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above, their contributions to the O(K4) Wilson coefficients are

cφR2 =
2T 2

e4v6

∑︂∫︂
N0

κ2φ,N0

(M
(D)
0,N0

)10
, (2.5.37)

caR2 = −caK4 = − 4T 2

e4v6

∑︂∫︂
N0

κ2a,N0

(M
(A)
0,N0

)8
, (2.5.38)

cBK4 = −2cBR2 =
8T 2

e4v6

∑︂∫︂
N2

κ2B,N2

(M
(D)
2,N2

)10
. (2.5.39)

To rewrite these spectral sums as radial integrals, we define

R3
(m=0)G

φ
1 = ζφXX , R2

(m=0)G
φ
2 = ζφXX , (2.5.40)(︁

−∂2r + 2f 2
)︁2
Ga = ζaXX , (2.5.41)

R3
(m=2)G

B
1 = ζBXX , R2

(m=2)G
B
2 = ζBXX . (2.5.42)

where R(m=0) and R(m=2) are the dilaton channel radial operators in the 0++ and 2+ sectors,

respectively, while the axion sector operator is −∂2r +2f 2. The spectral sums then reduce to

cφR2 =
4πT 2

e4v6

∫︂ ∞

0

dr r Gφ†
1 G

φ
2 , (2.5.43)

caR2 = −caK4 = −8πT 2

e4v6

∫︂ ∞

0

dr r Ga†Ga, (2.5.44)

cBK4 = −2cBR2 =
16πT 2

e4v6

∫︂ ∞

0

dr r GB†
1 GB

2 . (2.5.45)

We have thus reduced the full contributions of the three sectors to the O(K4) Wilson

coefficients to a set of radial integrals. In the next section, we evaluate these expressions

numerically and examine how the different massive sectors encode the dynamics of the ANO

string across the type-I, BPS, and type-II regimes.
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β eQa,0 evM
(A)
0,0 /

√
T

0.1 1.2432 0.4731

0.2 1.2353 0.4846

0.3 1.2295 0.4903

0.4 1.2266 0.4935

0.5 1.2204 0.4956

0.6 1.2148 0.4968

0.7 1.2114 0.4976

0.8 1.2046 0.4980

0.9 1.2013 0.4981

1.0 1.1967 0.4981

2.0 1.1333 0.4928

3.0 1.0841 0.4815

4.0 0.9807 0.4771

5.0 0.8974 0.4697

6.0 0.8107 0.4630

7.0 0.7274 0.4569

8.0 0.6433 0.4513

9.0 0.5587 0.4463

10.0 0.4787 0.4417

β eQφ,0 evM
(D)
0,0 /

√
T

0.1 1.8729 0.2148

0.2 1.5898 0.2813

0.3 1.4549 0.3280

0.4 1.3738 0.3649

0.5 1.3197 0.3956

0.6 1.2815 0.4218

0.7 1.2535 0.4447

0.8 1.2324 0.4648

0.9 1.2148 0.4823

1.0 1.1985 0.4977

1.1 1.1255 0.5101

1.2 1.0744 0.5219

1.3 1.0427 0.5372

1.4 1.0292 0.5404

Table 2.2: Numerical values of the couplings and masses, in units of
√
T , for the lowest

axion and dilaton bound states as functions of β for n = 1. Most spin-2 dilaton modes are

unbound over most of the β range. Here the physical tension and masses are T = τ(β) v2

and M ev.
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2.6 Numerical Results and Comparisons

In the previous section, we expressed the O(K4) Wilson coefficients as spectral sums over

the massive vortex modes. Physically, these coefficients measure how the massive modes of

the string affect the curvature response at long distance. Our goal here is to evaluate cR2

and cK4 numerically and understand how the different sectors, including both bound and

scattering states, contribute across the type-I, BPS, and type-II regimes. We then compare

our determination of the coefficients from the mode analysis with those derived using the

Born–Oppenheimer-like approach [1, 2]. We finally compare our results with the bounds on

the O(K4) Wilson coefficients from the flux-tube S-matrix bootstrap [3], placing the Abelian

Higgs model within the broader landscape of effective string theories, and comment on their

relation to existing results for Yang–Mills confining strings.

2.6.1 Numerical results

We focus here on the fundamental n = 1 string, for which the vortex is stable throughout the

full range of β considered. We evaluate the contributions of the bound states to the Wilson

coefficients cR2 and cK4 directly from their masses and eigenfunctions, or equivalently from

the corresponding couplings Q. The full spectral contributions, including both bound and

scattering states, are obtained using the completeness method of Sec. 2.5. An important

feature of the results below is that the contributions from scattering states are substantial

across a broad range of β, so both bound and scattering states are needed for a complete

description.

Figure 2.4 shows the dimensionless combinations of the Wilson coefficients, e4v2cR2 and

e4v2cK4 , as functions of β. 24 For cR2 , we show the total contribution from each massive sec-

tor, whereas for cK4 we further separate the contributions from bound states and scattering

states. The solid curves interpolate the numerical data. We now highlight the main features

24 Here the Wilson coefficients are written with their dependence on the microscopic parameters e and v
explicit. Below, we also express them in worldsheet units using the string tension T , which is more convenient
for the low-energy effective worldsheet theory.
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Figure 2.4: Decomposition of the Wilson coefficients for the fundamental n = 1 string. The

upper plot shows the contributions to cR2 from the 0++, 0−−, and 2+ sectors in blue, green,

and purple, respectively. The lower plot further separates the cK4 contributions into bound

states and scattering states: the 2+ scattering contribution is shown in purple, while the

0−− bound and scattering contributions are shown in dark and light green. The solid curves

interpolate the numerical data points. In both plots, the thick red curve gives the total

contribution from the massive sectors, while the nearly overlapping dotted curve shows the

Born–Oppenheimer result in [1, 2].
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of these results.

For cR2 , the positive 0++ dilaton contribution dominates in the strongly type-I regime and

competes with the negative contributions from the 0−− axion and 2+ sectors. As β increases,

the dilaton contribution decreases substantially, while the axion contribution becomes rel-

atively more important, causing the total cR2 to change sign. At large β, the coefficient is

dominated by the negative axion contribution.

For cK4 , only the 0−− axion and 2+ sectors contribute, both with positive sign. At small

β, the dominant contribution comes from the 2+ continuum.25 Its contribution decreases as

β increases, while the axion sector becomes progressively more important. Within the axion

sector, the contribution from bound states is largest around the BPS region, whereas the

contribution from scattering states grows toward large β and eventually dominates.

These trends are closely tied to the structure of the massive spectrum. In the type-

I regime, the Higgs is lighter than the vector, so the continuum threshold in the dilaton

channel is lower. This enhances the contribution of the dilaton-channel states, including the

spin-two continuum, and explains their importance at small β. As β increases, this relative

enhancement is lost and the axion sector becomes increasingly important.

The BPS point β = 1 provides a useful reference between the two regimes. Numerically,

the combination 2cR2 + cK4 vanishes within our numerical accuracy. The 2+ contribution

cancels identically in this combination, leaving only the 0++ dilaton and 0−− axion sectors.

The cancellation is particularly transparent for the bound states: at the BPS point, the

lightest dilaton and axion are degenerate and have equal couplings, as discussed in Sec. 2.4.3,

so their contributions to 2cR2 + cK4 cancel exactly. This cancellation is therefore consistent

with the special BPS structure of the theory and its supersymmetric embedding, in which

the string is half-BPS and the dilaton and axion are related by N = (0, 2) supersymmetry.

We will return to this point below when discussing β3 in the bootstrap picture.

25 For the fundamental n = 1 string, we find no 2+ bound state over the range of β considered.
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2.6.2 Comparison with the Born–Oppenheimer Approach

The O(K4) curvature corrections in the Abelian Higgs model were studied in Refs. [1, 2]

using a Born–Oppenheimer-like expansion of a weakly curved ANO vortex. In this approach,

the transverse vortex string profile is solved for in a slowly varying worldsheet geometry, and

its response to the curvature is then used to derive the effective worldsheet action.

The mode analysis developed here provides a complementary description of the same

low-energy curvature corrections. After converting the conventions of Refs. [1, 2] to ours, we

compare the resulting coefficients cR2 and cK4 .

As shown in Fig. 2.4, the two approaches show close numerical agreement over the full

range of β considered, with the dotted Born–Oppenheimer curve nearly overlapping the

result from the mode analysis. This provides a nontrivial check of the mode analysis. 26

At the same time, the mode analysis contains additional information: it resolves the

Wilson coefficients into contributions from the different massive sectors and further separates

the contributions from bound states and scattering states. This reveals how the underlying

dynamics controlling the curvature corrections evolves across different regimes of β.

2.6.3 Bootstrap Bounds and Comparison

Having determined the Wilson coefficients cR2 and cK4 , we can directly locate the ANO

strings within the allowed region of the flux-tube S-matrix bootstrap (β3, α3) parameter

space introduced in Sec. 2.1. For the ANO string, α3 and β3 are functions of β with a

common overall factor of 1/e4. Thus, at fixed e, varying β traces out a trajectory in the

bootstrap plane, while varying e radially rescales it. Figure 2.6 shows this trajectory at e = 1

for illustration. 27 The main features are as follows:

26By the result of [1, 2] we mean values obtained numerically using the formulas developed there, evaluated
at the values of β considered here. At the points also considered in [1, 2], the values agree with those reported
there, as expected.

27 Although this value is not parametrically weakly coupled, it provides a convenient normalization for
displaying the result.
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Figure 2.5: Wilson coefficients α3 and β3 of the fundamental n = 1 ANO string as β is varied.

As β increases, α3 decreases, while β3 increases and changes sign at the BPS point β = 1.

At larger β, both coefficients vary more slowly and appear to approach constant values.

• As β increases, α3 decreases, while β3 increases and changes sign at the BPS point.

Since β3 ∝ −(2cR2 + cK4), this crossing reflects the BPS cancellation discussed above.

The type-I regime lies on the left side of the bootstrap plane, the BPS string lies on

the line β3 = 0 up to numerical accuracy, and the type-II regime lies on the right. At

larger β, both coefficients vary more slowly, suggesting that the ANO string trajectory

approaches a limiting point over the range shown.

• The bootstrap boundary has two characteristic branches. The right branch is associ-

ated with a sharp worldsheet axion resonance, while the left branch is associated with

a sharp dilaton resonance [3, 4]. The ANO trajectory follows the same qualitative

pattern: the type-I regime lies on the dilaton side, the BPS point crosses β3 = 0, and

the type-II regime moves to the axion side. This is consistent with the level crossing

of the lightest dilaton and axion masses at the BPS point.

• Varying e instead radially rescales the trajectory. In the weakly coupled regime, the

common factor 1/e4 makes the coefficients grow as e is decreased, while increasing e

moves the trajectory toward the origin. At sufficiently strong coupling, however, the

semiclassical calculation is no longer under perturbative control.
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Figure 2.6: Fundamental n = 1 ANO strings in the (β3, α3) bootstrap parameter space. The

blue shaded region is the allowed region [3, 4], bounded by the dilaton branch on the left

and the axion branch on the right. The left plot shows the ANO trajectory as β is varied

at e = 1, with type I strings on the left, the BPS point at β3 = 0, and type II strings on

the right. The right plot zooms in near the origin, where the SU(3) and SU(5) Yang–Mills

estimates lie close to the axion branch.

2.6.3.1 Comparison with Yang–Mills Flux Tubes

It is natural to compare ANO strings with Yang–Mills flux tubes. Such a comparison is

motivated by the long-standing dual superconductor picture of confinement, in which con-

fining electric flux tubes are viewed as electric–magnetic duals of ANO vortices [41, 42]. In

particular, this picture is realized explicitly in Seiberg–Witten theory, where a soft breaking

to N = 1 leads to monopole condensation and confinement, described at low energies by

an Abelian Higgs theory [43, 44]. This provides a controlled setting in which the relation

between confining flux tubes and ANO vortices can be studied explicitly.

At the level of the effective worldsheet theory, the two systems can be compared in the

(α3, β3) plane. The SU(3) and SU(5) points shown along the axion branch in Fig. 2.6

schematically indicate where the corresponding Yang–Mills flux tubes may lie in the boot-
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strap parameter space. This is motivated by lattice measurements of the worldsheet axion,

whose mass and coupling are closely matched by the axion resonance on this branch [3, 4].

The Yang–Mills theories lie on the same side of the allowed region as type II ANO

strings, consistent with both supporting a relatively light worldsheet axion. However, their

string dynamics are quite different: type II ANO strings repel, whereas Yang–Mills confining

strings attract and form bound states. This difference creates a tension with the duality,

which would suggest broader agreement in the spectrum and string interactions. In this

sense, the minimal Abelian Higgs model does not provide a direct microscopic description

of the Yang–Mills confining string.

It is worth emphasizing that the Abelian Higgs model captures only a subsector of the

softly broken Seiberg–Witten theory. In the full supersymmetric theory, additional bosonic

and fermionic fields are present, and these may significantly modify the string dynamics.

It would therefore be interesting to extend the present analysis to the full supersymmetric

theory and explore the duality from the worldsheet perspective.

2.6.4 n > 1 strings

Our analysis has focused on the fundamental n = 1 string, for which the string is stable and

the translational Goldstones are the only massless worldsheet degrees of freedom throughout

the range of β considered. For n > 1, the situation depends qualitatively on the regime of

β.

In the type-I regime, higher-winding strings are stable, so the mode analysis can be

extended to construct a well-defined effective string theory. As n increases, the Wilson

coefficients become larger at fixed β and e, moving the ANO string points upward in the

bootstrap parameter space. In the type-II regime, by contrast, these strings contain tachy-

onic fluctuation modes, indicating an instability toward splitting into fundamental vortices.

Consequently, there is no well-defined low energy effective action.

At the BPS point, higher-winding strings possess additional zero modes associated with
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the relative positions of the fundamental strings. The low-energy worldsheet theory must

therefore include these additional moduli and cannot be described solely in terms of the two

translational Goldstones. It would be interesting to study this enlarged effective action.
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CHAPTER 3

Non-Invertible Symmetries in SN Orbifold CFTs and

Entanglement Entropy

3.1 Introduction

In recent years, generalized and non-invertible symmetries in various dimensions have been a

very active field of investigation [14–16, 45–98] providing valuable insight into the dynamics of

quantum field theories. At the core of these generalizations is the realization of symmetries

as (extended) topological operators and vice versa. In this picture, a natural question is

to find the holographic dual of these symmetry operators in the bulk. In theories with

weakly coupled holographic duals, it has been proposed that boundary topological operators

correspond to D-branes in the bulk [99–113] which, in certain limits, can become topological.

These proposals are based on anomaly inflow arguments. The goal of this paper is to put

forward a proposal for the holographic dual of topological operators in a setup with a strongly

coupled bulk theory using the AdS3/CFT2 correspondence.

In two-dimensional conformal field theories (CFT), non-invertible symmetries have a

long history starting with the work of Verlinde in rational CFTs [114], the construction of

topological defects in terms of projectors [115, 116], the construction of topological duality

defects [117, 118], and the topological field theory formulation of RCFTs [119] to name a few.

Orbifolds are a powerful way to obtain new CFTs from old ones [120, 121]. In this paper,

we focus on the so-called symmetric orbifold CFT, where one takes the tensor product of N

copies of a seed CFT M and gauges the SN symmetric group [17] that permutes the different

copies. A remarkable feature of these theories is that they observe a large-N factorization of

58



correlation functions [122–124], similar to the case of single-trace operators in large-N gauge

theories. Proposals for the holographic dual of symmetric orbifold CFTs go back to [125],

relating a type IIB AdS3 × S3 × M4 background, with M4 being either K3 or T 4, to the

N = (4, 4) supersymmetric orbifold CFT M⊗N
4 /SN . This background allows for an exact

worldsheet description with only NS-NS flux. However, it has been a challenge to identify

the particular background which corresponds to the undeformed M⊗N
4 /SN orbifold [126].

Recently, such a dual was found for the AdS3×S3×M4 background with the minimal k = 1

unit of NS-fivebrane flux [18–21, 127].

It is well known that gauging a group-like symmetry leads to a quantum symmetry in the

gauged theory [128, 129]. Hence, by construction, an orbifold CFT exhibits a universal set

of symmetries arising by the gauging of a discrete group. In the case of interest, the gauging

of the non-abelian SN group leads to a universal set of non-invertible symmetries. In this

work, we look at these universal defects in two-dimensional symmetric orbifold CFTs. We

construct them by applying the projector construction of Petkova and Zuber [115], and use

the modular transformations of the partition function to identify the defect Hilbert spaces

of operators on which line-defects can end. Additionally, we propose a realization of the

defect operators in terms of non-gauge invariant operators under SN . These defects, being

universal, depend solely on the group theory structure of SN and not on the specifics of

the seed CFT. To illustrate their properties, we examine the simplest example that exhibits

non-invertible symmetries, i.e. N = 3.

In symmetric orbifold CFTs, universal defects are labeled by the representations of SN .

We study these defects in the large-N limit and analyze which representations remain non-

trivial. We argue that these defects correspond to topological defects on the worldsheet and

propose an explicit realization. While we verify some of their properties, further investigation

is required for a complete realization.

The structure of this chapter is as follows: In section 3.2, we review some background

material, in particular non-invertible symmetries in RCFTs and the construction of symmet-

ric orbifold CFTs. In section 3.3, we construct the universal topological line-defect operators
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in the symmetric orbifold CFTs that realize the Rep(SN) fusion algebra. We use the mod-

ular transformation of the torus partition function with a defect inserted to determine the

corresponding defect Hilbert spaces, and we construct the vacuum-state operators in terms

of non-gauge invariant twist fields. In section 3.4, we present a detailed example of the S3

symmetric orbifold. This is one of the simplest examples where non-invertible symmetries

arise in CFTs. We determine the lines and defect operators, as well as the Ward identities for

two and three-point correlators of twist operators. In section 3.5, we discuss non-universal

topological defects, starting with a nontrivial topological defect operator in the seed theory

and constructing a “maximally fractional” defect, where all sectors are built on the same

seed CFT defect in an SN invariant manner. We show that such defects are consistent, in

the sense that they satisfy the Cardy-Petkova-Zuber [115, 116, 130] conditions. In section

3.6, we discuss some aspects of the large-N limit of these defects, particularly whether a

non-invertible defect survives this limit. In section 3.7, we discuss the AdS/CFT dual of

the symmetric orbifold [20], which states that the AdS dual is a type IIB string theory on

AdS3 × S3 ×M4 with one unit of NS-NS fivebrane flux. We propose a worldsheet dual of

the universal defects and discuss some of their properties. In section 3.8, we calculate the

entanglement entropy in the presence of universal and non-universal topological defects. In

section 3.9, we close with some discussion of our results and list some open questions and

speculations.

3.2 Review

In this section, we review well-known material which will play an important role in the main

part of the paper. First, we discuss the construction of Verlinde lines in rational confor-

mal field theories, introducing key concepts of non-invertible symmetries in two-dimensional

CFTs. Second, we review the construction of the M⊗N/SN symmetric orbifold CFT, for

which we will construct the non-invertible symmetries in following sections.
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3.2.1 Non-invertible symmetries in rational CFTs

Let us first look at the construction of topological line-defects in rational conformal field

theories (RCFTs). We will restrict our attention to the case of diagonal RCFTs and the

Verlinde lines [114] which are in one-to-one correspondence with the chiral primaries. The

torus partition function of such an RCFT is given by

Z(τ, τ̄) =
∑︂
i,j

nij χi(τ)χ̄j(τ̄) , (3.2.1)

where nij = δij and χi(τ) denotes the character of a finite irreducible chiral algebra labeled

by the representation i. Under the modular S-transformation, the characters transform as

χi(−1/τ) =
∑︁

j Sij χj(τ). The operator corresponding to a Verlinde line Ia associated to the

chiral primary |Φa⟩ is given by [115, 116]

Ia =
∑︂
i

Sai
S0i

Pīi , (3.2.2)

where Pīi is a projector acting on the space spanned by the i-th primary and its descendants:

Pīi =
∑︂
nn̄

|i, n⟩ ⊗ |i, n̄⟩ ⟨i, n| ⊗ ⟨i, n̄| . (3.2.3)

Using the Verlinde formula [114],

ncab =
∑︂
i

Sai Sbi S
∗
ci

S0i

, (3.2.4)

we can verify that the fusion algebra of the Verlinde lines is isomorphic to that of the chiral

primaries,

Ia Ib =
∑︂
c

ncab Ic , (3.2.5)

where ncab is the non-negative integer fusion coefficient, which denotes the multiplicity with

which Ic appears in the fusion product of the defects. Given that the Verlinde lines act as

projectors on the modules of the chiral algebra, which includes the Virasoro algebra, they

commute with both the holomorphic and anti-holomorphic modes of the stress tensor,

Ln Ia = Ia Ln , L̄n Ia = Ia L̄n , (3.2.6)
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and are therefore topological. Using the folding trick of [131, 132], the topological defects

have a realization as Ishibashi boundary states [130, 133] which characterize Z2 permutation

branes [134–136]. If we start with the folded theory CFT(1) × CFT(2), the boundary state

defining a Z2 permutation brane is given by

| Ba⟩⟩ =
∑︂
i

Sai
S0i

∑︂
n

|i, n⟩(1) ⊗ |i, n⟩(2)
∑︂
m

|i,m⟩(2) ⊗ |i,m⟩(1) , (3.2.7)

such that they obey the following Virasoro gluing conditions:(︂
L
(1)
k − L̄

(2)
−k

)︂∑︂
n

|i, n⟩(1) ⊗ |i, n⟩(2) = 0 ,(︂
L
(2)
k − L̄

(1)
−k

)︂∑︂
m

|i,m⟩(2) ⊗ |i,m⟩(1) = 0 .

The quantum dimension of the topological defect operator is the eigenvalue of the defect

acting on the CFT vacuum state,

Ia |0⟩ = ⟨Ia⟩ |0⟩ . (3.2.8)

For the Verlinde lines we obtain ⟨Ia⟩ = Sa0/S00. It was pointed out in [14] that defects that

have a quantum dimension not equal to one are in general associated with non-invertible

symmetries. Note that in the boundary state representation (3.2.7) the quantum dimension

is obtained by ⟨Ia⟩ = ⟨0 | Ba⟩⟩.

Operators like (3.2.2) satisfying the Cardy-Petkova-Zuber [115, 116, 130] conditions can

be viewed as topological line-defects. The action of these line-defects can be visualized on

the complex plane mapped from the cylinder as in Figure 3.1, where we insert the defect at

a particular point in time. We refer to the Hilbert space defined on S1 for every point in

time as the untwisted Hilbert space.

The corresponding torus partition function is given by inserting the defect inside the

trace over the Hilbert space,

Za(τ, τ̄) = trH[Ia qL0−
c
24 q̄L̄0−

c
24 ] , (3.2.9)

where q = e2πiτ with τ being the torus modular parameter. After performing a modular

S-transformation, the line-defect now extends in the time direction, and at every point in
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Ia

|O⟩ ∈ H

Ia
O(x)

Figure 3.1: Using the state-operator correspondence to depict the action of the line-defect

on an operator in the untwisted Hilbert space.

time we obtain the defect Hilbert space, HIa . The torus partition function is now modified

to trace over this defect Hilbert space corresponding to the defect Ia,

Za(− 1
τ
,− 1

τ̄
) = trHIa

[q̃L0−
c
24 ¯̃qL̄0−

c
24 ] , (3.2.10)

where q̃ = e−2πi/τ . Using the S-transformation of the characters, and the fact that the defect

commutes with the chiral vertex algebra, we can expand the defect Hilbert space in terms

of the characters. The defect partition function can thus be written as

Za(τ, τ̄) =
∑︂
b,c

N c
ab χb(τ)χ̄c(τ̄) , (3.2.11)

where the non-negative integers N c
ab encode the degeneracy of the states in HIa . Note that

even though we started with a diagonal theory, the defect partition function is not necessarily

diagonal, i.e. N c
ab need not be a diagonal matrix. This tells us that states in HIa have non-

integer spins and correspond to non-local operators attached to the corresponding line Ia.

Ia

|Ψ⟩ ∈ HIa

Ia

Ψ(x)

Figure 3.2: States in the defect Hilbert space HIa correspond to non-local operators attached

to the line-defect Ia.

An important feature of non-invertible line-defects is the “lasso” effect [14] where, when a

topological line-defect is moved past a local operator, one obtains in addition to the symmetry

63



action on the local operator another topological line ending on a defect operator and a

junction of topological line operators (see Figure 3.3). The mathematical structure describing

symmetry line-defects, defect operators, and their manipulations is called a tube algebra [68].

O
I =

1

dim I

⎛⎜⎜⎜⎝ I · O
I

⎞⎟⎟⎟⎠+ Odefect

I

I

Figure 3.3: Lasso action of a topological line-defect.

3.2.2 Symmetric Orbifold CFT

In this section, we review the symmetric orbifold CFT. Consider N copies of a CFT M

(not necessarily rational). The tensor product CFT has an SN symmetry that permutes

the N copies of the theory. We construct the SN orbifold CFT by gauging this permutation

symmetry. Let’s denote the primary operators of the tensor product theory by OI where I =

1, 2, . . . , N . The spectrum of the orbifold theory consists of the untwisted sector constructed

by taking gauge invariant combinations of operators in the tensor product theory such as

N∑︂
I=1

OI ,
N∑︂

I,J=1

OIOJ , . . . . (3.2.12)

Modular invariance additionally requires twisted sectors. We introduce the twist operators

σg labeled by the elements of SN by

OI(e
2πiz) σg(0) = Og·I(z) σg(0) . (3.2.13)

These operators introduce non-trivial holonomies for the operators of the seed theory. How-

ever, the operators σg are not gauge invariant. To define gauge invariant operators we define

[123, 124, 137]

σ[g] ∝
∑︂
h∈SN

σh−1gh , (3.2.14)
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labeled by the conjugacy classes [g] of SN . The proportionality constant can be fixed by

normalizing the two-point function of these operators [124]. A conjugacy class [g] is fixed by

giving the number li of cycles of length i = 1, 2, · · ·N .

[g] = 1l1 · 2l2 · · ·N lN ,
∑︂
k

k lk = N . (3.2.15)

Excited states are created by acting with operators of the seed theory on twisted states. For

example, consider the non-gauge invariant twist operator σg where g is a cycle of length n.

Given (3.2.13), the operators of the seed theory have fractional modes

OI(z) =
1

n

∑︂
m

(OI)m
n
z−

m
n
−hOe−2πim

n
(I−1) . (3.2.16)

The modes with fractional indices correspond to excited twist operators. Hence, in the

twisted sector corresponding to an element of SN with a single cycle of length n, there are

n subsectors (the vacuum twist operator σn and exited states dressed with fractional modes

of the operators of the seed theory). More generally, in a twisted sector created by σg,

twist operators are labeled by the centralizer of g. Thus, the torus partition function can be

written as follows [137, 138]

Z =
1

|G|
∑︂
gh=hg

h
g

(τ, τ̄) , (3.2.17)

where g denotes the twisted sector and h an element of its centralizer. Each term in the sum

is equal to

h
g

(τ, τ̄) = trHg

(︂
h e2πiτ(L0− c

24
) e−2πiτ̄(L̄0− c

24
)
)︂
. (3.2.18)

The summation of elements h ∈ SN that commute with g imposes the projection onto states

that are invariant under the centralizer C[g]. Here |G| = N ! is the order of SN . Using the

fact that the torus partition function in the individual sectors transforms as follows under

modular transformations τ → − 1
τ

h
g
(τ, τ̄) → g−1

h

(−1

τ
,−1

τ̄
) , (3.2.19)
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it is straightforward to check that the orbifold partition function is modular invariant.

The spectrum of the twisted sectors can be obtained by expanding the partition function.

For a twisted sector labelled by a cycle [g] in (3.2.15), the conformal dimensions hCFT of the

universal twisted sector ground state is given by

hCFT =
N∑︂
k=1

lk
cseed
24

(︁
k − 1

k

)︁
. (3.2.20)

These operators do not depend on the details of the seed CFT. In addition, there are twisted

sector states built on primaries in the seed theory with hseed > 0 as well as (fractional)

Virasoro descendants, but these states will not play an important role in the following.

Another way [17, 139] to look at the partition function is via a grand canonical generating

function. The modular invariant partition function of the seed theory is denoted as Z(τ, τ̄)∑︂
N

pNZN = exp[
∞∑︂
k=1

pkTkZ(τ, τ̄)] , (3.2.21)

where Tk is the Hecke operator

TkZ(τ, τ̄) =
1

k

∑︂
i|k

i−1∑︂
j=0

Z
(︂kτ
i2

+
j

i
,
kτ̄

i2
+
j

i

)︂
. (3.2.22)

Correlation function of twist operators can be calculated by going to the covering space [121,

123, 124, 140, 141]. Suppose we want to calculate a correlation function of twist operators.

Due to (3.2.13), correlation functions of non-gauge invariant operators have branch cuts. The

union of the different sheets forms the covering space. Although we consider the orbifold

theory on S2, the covering space does not necessarily have zero genus; its genus is determined

by the Riemann–Hurwitz formula [123].

3.3 Universal defects in symmetric orbifolds

We construct the orbifold CFT starting with a tensor product of N copies of a seed theory

M and gauge the SN symmetry that permutes the N copies. The gauged theory exhibits

a quantum symmetry Rep(SN)1 [47, 128, 129]. In this section, we construct these universal

1Intuitively, this symmetry is generated by the Wilson lines of the SN gauge field.
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topological defects using the projector construction of Petkova and Zuber [115]. In particular,

the details of the seed CFT will not play a role in the sense that the defect can be thought

of as being built on the trivial topological defect in the seed CFT, which always exists. In

addition to these defects, there may be other topological defects coming from the defects

of the seed theory itself. We discuss non-universal defects, which are based on nontrivial

topological defects in the seed theory, in section 3.5.

3.3.1 Construction

Utilizing the folded permutation brane construction for a topological defect, a universal

defect corresponds to the following boundary state in the folded M⊗N/SN ×M⊗N/SN CFT

| BR⟩⟩ =
∑︂
[g]

χR([g])
∑︂
n

| n⟩(1),[g] ⊗ | n⟩(2),[g]
∑︂
m

| m⟩(2),[g] ⊗ | m⟩(1),[g] , (3.3.1)

Here [g] denotes the twisted sector in the M⊗N/SN orbifold labeled by the conjugacy class

of SN . The summation over n,m denotes the sum over all states in the [g]-twisted sector

including the sum over primaries of the seed theory as well as Virasoro descendants producing

an Ishibashi boundary state [133]. The folded boundary state, and thus the defect, is labeled

by the choice of representation R of SN with χR([g]) being the character of the conjugacy

class [g] in the representation R. Consequently, the boundary state satisfies(︂
L(1)
n − L̄

(2)
−n

)︂
| BR⟩⟩ =

(︂
L(2)
n − L̄

(1)
−n

)︂
| BR⟩⟩ = 0 , (3.3.2)

where L(i)
n , i = 1, 2 are the modes of the stress tensor of the two copies of the M⊗N/SN

orbifold after folding. After unfolding, the two copies of the CFT living on half-spaces are

separated by the defect operator

IR =
∑︂
[g]

χR([g])P[g]P̄[g] . (3.3.3)

The defect is expressed in terms of the identity projectors in the [g]-twisted sector satisfying

P 2
[g] = P[g] and P[g]P[g′] = 0 if [g] ̸= [g′]. It is clear from the property of the projectors or
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the unfolding of the boundary state condition (3.3.2) that the defect is topological, i.e. it

commutes with the holomorphic and anti-holomorphic modes of the stress tensor separately.

Ln IR = IR Ln , L̄n IR = IR L̄n . (3.3.4)

Using the properties of the projection operators, one can calculate the fusion product of two

defect operators labeled by two representations R1,2

IR1IR2 =
∑︂
[g]

χR1([g])χR2([g])P[g]P̄[g]

=
∑︂
R3

1

|G|
∑︂
g

χR1(g)χR2(g)χR3(g)
∗IR3

=
∑︂
R3

NR3
R1R2

IR3 . (3.3.5)

Here NR3
R1R2

are the Kronecker coefficients of the decomposition of the tensor product R1⊗R2

into representations R3. Since SN for N > 2 is a non-abelian group, the topological line-

defects include non-invertible ones. This can also be seen from the fact that acting on a

state in the [g]-twisted sector one has

IR | Φ[g]⟩ = χR([g]) | Φ[g]⟩ . (3.3.6)

In particular, this implies that the quantum dimension of a defect IR is given by ⟨IR⟩ =

χR(1) = dimR, i.e. the dimension of the representation. In general, for SN with N > 2,

apart from the trivial and the alternating (or sign) representation, all other representations

have dimensions greater than one, hence giving rise to non-invertible defects.

3.3.2 Modular invariance and defect operators

In this section, we use modular invariance to identify the operators in the defect Hilbert

space which can end on topological lines. The starting point is to insert a defect IR along

the spatial cycle in the torus partition function
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ZR(τ, τ̄) =
1

|G|
∑︂
gh=hg

trHg

(︂
h e2πiτ(L0− c

24
) e−2πiτ̄(L̄0− c

24
) IR

)︂
=

1

|G|
∑︂
gh=hg

χR([g]) h
g

(τ, τ̄) . (3.3.7)

The defect Hilbert space can be obtained by performing a modular transformation τ → − 1
τ
=

τ ′, which exchanges the spatial and temporal cycles. Using the modular transformation

(3.2.19), the defect partition function is given by

ZR(τ
′, τ̄ ′) =

1

|G|
∑︂
gh=hg

χR([g]) g

h

(τ ′, τ̄ ′) , (3.3.8)

where we used the fact that the characters of SN are real.

In the orbifold partition function, we decompose the elements h, g which commute gh =

hg by labeling the element g by its conjugacy class and h by the element of the centralizer.

However, one can do this the other way around, where h labels conjugacy classes and g labels

the centralizer of h.

The simplest and most relevant case to the large-N limit is when h corresponds to a

single cycle of length [w]. The centralizer of such an element is Zw × SN−w. The group Zw

contains elements 1, ω, ω2, · · ·ωw−1, where ω is the w-th root of unity. The defect partition

function corresponding to the single w-twisted cycle can be written as

ZR,[w] =
1

dimC[w]
χR(C[w]) C[w]

[w]

. (3.3.9)

Using the decomposition of C[w] = Zw × SN−w and dimC[w] = w(N − w)!, one gets

ZR,[w] =
1

(N − w)!

∑︂
g∈SN−w

1

w

(︂
χR([1w × g]) 1w × g

[w]

+
w−1∑︂
k=1

χR([ω
k × g]) ωk × g

[w]

)︂
.

(3.3.10)

To determine the number of defect operators, we want to pick out the ground state

contribution of the w-twisted sector from (3.3.10), which has the conformal dimension

h = h̄ =
cseed
24

(︁
w − 1

w

)︁
. (3.3.11)
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As far as the SN−w permutation is concerned, the sector [w] is untwisted. Consequently, the

insertion of g ∈ SN−w contributes the same factor to the ground state in the defect partition

function (3.3.10). The same holds for the 1w and ωk, k = 1, 2, · · ·w− 1 insertions since these

enforce the h− h̄ ∈ Z projection, which is automatically satisfied for the twisted ground state

(3.3.11). This implies that the number of w-twisted defect ground states is simply obtained

by setting □ = 1 for all terms in the partition function (3.3.10), giving

nRw =
1

(N − w)!

∑︂
h′∈SN−w

1

w

w−1∑︂
k=0

χR([ω
k × h′]) , (3.3.12)

where we included ω0 = 1w. A vanishing nRw implies that the IR defect cannot end on a bare

twist operator in the w-twisted sector.

One way to understand the defect operators at the endpoints of topological line-defects

is to view these line-defects as open Wilson lines ending on non-gauge invariant operators

[129]. A natural proposal for such operators involves using characters to project onto the

representation R

σRg ≡ NR

∑︂
h∈SN

χR(h) σh−1gh , (3.3.13)

where we pick an element g in the conjugacy class that labels the twisted sector and we

focus again on a single cycle of length w. We propose that the IR line-defect can end on a

defect operator in the [g]-twisted sector if (3.3.13) does not vanish. We can decompose the

sum over h ∈ SN in (3.3.13) into a sum over the centralizer of g and the rest

σRg ≡ NR

(︂ ∑︂
h′∈SN−w

w−1∑︂
k=0

χR([ω
k × h′])σg + · · ·

)︂
, (3.3.14)

where the dots denote summation over other group elements in the conjugacy class of g.

Note that the coefficient multiplying σg in (3.3.14) is proportional to (3.3.12). Consequently,

the vanishing of one implies the vanishing of the other and the criterion for the existence of

a defect operator ending on a line-defect is the same. The vanishing of all the terms on the

right-hand side of (3.3.13) can be established by conjugating the group element g and using

the fact that the characters take the same value on all elements of the same conjugacy class.
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It should be noted that for SN with N > 4, the degeneracy of the twisted sector ground

states (3.3.12) can be larger than one. For the non-gauge invariant operators in (3.3.13), this

can be understood by the fact that the action of SN on all elements g in a fixed conjugacy

class by conjugation g → h−1gh determines a (generally) reducible representation. The value

nRw gives the number of times the irreducible representation R appears in this representation.

In the next section we will further test this construction by evaluating correlation func-

tions of defect operators and check the Ward identities following from the non-invertible

symmetry Rep(S3).

3.4 Example: S3 symmetric orbifold

We now consider a simple example, the S3 orbifold theory of a seed CFT M with central

charge c. Upon gauging the S3 symmetry, a Rep(S3) quantum symmetry emerges. The

objects of Rep(S3) symmetry are topological lines which are labeled by the irreducible rep-

resentations of S3.

The symmetric group S3 is a non-abelian group consisting of permutations of three ele-

ments. The group-elements of S3 are

S3 = {e, (12), (23), (31), (123), (132)} , (3.4.1)

where e is the identity permutation, (12) is a 2-cycle representing the permutation 1 → 2 → 1,

(123) is a 3-cycle representing the permutation 1 → 2 → 3 → 1 and so on. There are three

conjugacy classes

[e] = {e}, [2] = {(12), (13), (23)}, [3] = {(123), (132)} . (3.4.2)

The character table of S3 is given below

[e] [2] [3]

χe 1 1 1

χA 1 −1 1

χS 2 0 −1

(3.4.3)
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where e denotes the trivial representation, A denotes the alternating representation, and S

denotes the standard representation.

In this case, the fusion rules of the universal defects defined in (3.3.3) follow from the

above character table and read

IA × IA = 1,

IS × IA = IA × IS = IS,

IS × IS = 1 + IA + IS . (3.4.4)

We see that the line-defect associated with the standard representation is non-invertible.

Using (3.2.14), the gauge invariant ground state operators are

σ[2] =
1√
3

(︂
σ(12) + σ(23) + σ(13)

)︂
,

σ[3] =
1√
2

(︂
σ(123) + σ(132)

)︂
, (3.4.5)

where the proportionality constants were fixed by requiring that the two-point functions be

normalized to 1. The action of the defects on these operators is summarized in Figure 3.4.

σ[2]
= − σ[2]

σ[3]
= σ[3]

σ[2]
= 0

σ[3]
= − σ[3]

Figure 3.4: Action of the universal line-defects. The red line denotes the invertible sign

defect IA while the black line denotes the standard defect IS.

Next, let us discuss the defect Hilbert spaces. From (3.3.13), we observe that there are

no two-cycle ground states in HIA and no three-cycle ground states in HIS . The twisted
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ground states in the defect Hilbert space are

σS[2] = NS

(︂
2σ(12) − σ(23) − σ(13)

)︂
,

σA[3] = NA

(︂
σ(123) − σ(132)

)︂
. (3.4.6)

Here, without loss of generality, we choose σ(12) and σ(123) as representatives of [2] and [3] re-

spectively. The constants NA, NS can be fixed by normalizing the two-point correlators of the

non-gauge invariant operators with the line-defects inserted to 1. For example, demanding

that

⟨ σS[2] σS[2] ⟩ = N2
S

(︂
4⟨σ(12)σ(12)⟩+ ⟨σ(23)σ(23)⟩+ ⟨σ(13)σ(13)⟩

)︂
= 6N2

S = 1 ,
(3.4.7)

gives us N2
S = 1/6. Similarly, we get N2

A = −1/2. To show this, we used that the two-point

correlator vanishes unless the permutation corresponding to the second twist operator is the

inverse of the first [123]. In the above correlator, we implicitly assumed that insertions of

the two operators are at the poles of the sphere.

Next, we determine the coefficients in the lasso diagrams. Since the defects are topo-

logical, the scaling dimension does not change and the two possible diagrams are shown in

Figure 3.5. In the following, we fix the coefficients α and β.

σ[2]
= α

σS[2]

σ[3]
= β

σA[3]

Figure 3.5: Lasso diagrams where the right-hand side is obtained after shrinking the standard

defect loop which produces a defect operator.
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= 1
2 + 1

2
+ 1√

2

= 1
2 + 1

2
− 1√

2

= 1√
2

− 1√
2

Figure 3.6: F-symbols of Rep(S3) .

Consider the two-point correlator of the two-cycles encircled by the IS line. We can

shrink the line-defect to a point by avoiding both operators, which gives us the quantum

dimension of the line ⟨IS⟩. Alternatively, we can make use of the F-symbols [142, 143] in

Figure 3.6 corresponding to the crossing relations of Rep(S3) to pull the line-defect through

the operators and then shrink it to a point. Pictorially, the two ways of shrinking the defect

are

⟨σ[2] σ[2]⟩ = 1
dimS

⟨ σ[2] σ[2] ⟩ = 1
2
√
2
⟨ σ[2] σ[2] ⟩ = α2

2
√
2
⟨ σS[2] σS[2] ⟩ ,

(3.4.8)

Requiring that the correlators on both sides are normalized to 1, we get α2 = 2
√
2. Similarly,

for the two-point correlator of the three-cycle ground states,

⟨σ[3] σ[3]⟩ = 1
dimS

⟨ σ[3] σ[3] ⟩ = 1
4
⟨ σ[3] σ[3] ⟩+ 1

4
⟨ σ[3] σ[3] ⟩

= 1
4
⟨σ[3] σ[3]⟩+ β2

4
⟨ σA[3] σA[3] ⟩ , (3.4.9)
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leads to β2 = 3.

We can now obtain selection rules for the three-point correlators in the presence of

the line-defects. The only non-trivial three-point correlators of bare twist operators are

⟨σ[2]σ[2]σ[3]⟩ and ⟨σ[3]σ[3]σ[3]⟩. To illustrate the procedure we focus on the former. As in the

case of two-point functions, the locations of the operators in the three-point correlators are

fixed using the SL(2,R) symmetry. Consider a line-defect IS encircling only σ[3]. This is

equivalent to encircling both the σ[2] operators on the sphere as illustrated in Figure 3.7.

The second line in the figure is obtained by using the F-symbols in Figure 3.6 and the lasso

diagram in Figure 3.5. The correlator ⟨σ[2]σ[2]σ[3]⟩ can be expanded using (3.4.5) as follows

−
σ[2] σ[2]

σ[3]
=

σ[2] σ[2]

σ[3]
=

σ[2] σ[2]

σ[3]

= 1√
2

σ[2] σ[2]

σ[3]
= 2

σS[2] σS[2]

σ[3]

Figure 3.7: The Ward identity associated with IS wrapping σ[3]. We can shrink the line-

defect the other way on the sphere which gives the correlator with both the σ[2] encircled.

−⟨σ[2]σ[2]σ[3]⟩ =
−1

3
√
2
⟨ (σ(12) + σ(23) + σ(13))(σ(12) + σ(23) + σ(13))(σ(123) + σ(132)) ⟩

= −
√
2 C223 , (3.4.10)

where we have defined C223 ≡ ⟨σ(12)σ(23)σ(123)⟩ = ⟨σ(12)σ(13)σ(132)⟩ = ⟨σ(23)σ(13)σ(123)⟩. Mean-

while, the rightmost correlator in the second line of Figure 3.7 can be computed using (3.4.6)

as

2⟨σS[2] σS[2] σ[3]⟩ = 2
1

6

1√
2
⟨(2σ(12) − σ(23) − σ(13))(2σ(12) − σ(23) − σ(13))(σ(123) + σ(132))⟩

= −
√
2 C223 = −⟨σ[2]σ[2]σ[3]⟩ . (3.4.11)
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Hence, using the explicit expressions of non-gauge invariant twist fields, we can check the

Ward identity of IS. Similarly, we can also use these defects to calculate the following

correlator

σS[2] σS[2]

σA[3]

= −
√
3
2
⟨σ[2]σ[2]σ[3]⟩ .

(3.4.12)

σ[2] σ[2]

σ[3]
= 1

2

σ[2] σ[2]

σ[3]
= α2

4

σS[2] σS[2]

σ[3]

= − α2

4
√
2

σS[2] σS[2]

σ[3]
−α2β

4
√
2

σS[2] σS[2]

σA[3]

Figure 3.8: The Ward identity associated with IS encircling all three operators giving rise to

a junction. Shrinking the line-defect by avoiding the operator insertions gives us ⟨IS⟩ = 2.

3.5 Non-universal defects

In section 3.3, we constructed universal defects labeled by an irreducible representation R

of the symmetric group SN . As can be seen from the expression (3.3.3), the defect operator

in each twisted sector is proportional to the identity operator and hence does not depend on

the details of the seed CFT. Another way to look at this is that the topological defect one

starts with, in the seed theory, is the identity or trivial defect. It is an interesting question

whether one can start with a nontrivial defect in the seed theory and construct non-universal

defects which depend on the details of the seed theory and the topological defects present in

it. Similar questions arise in the construction of D-brane states in symmetric orbifolds, as

discussed in [144, 145], which we will build upon in the following section.
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Here we only construct a simple example of a non-universal defect that is analogous to

the “maximally fractional” D-brane of [144]. A twisted sector (3.2.15) in the SN orbifold

theory is labeled by a conjugacy class [g] which is fixed by giving the number li of cycles of

given length i = 1, 2, · · ·N . We focus on diagonal RCFTs discussed in section 3.2.1 as the

seed CFT. In particular, we use the defects Ia in the RCFT defined in (3.2.2). In the tensor

product states, we will use the same boundary state labeled by a for all factors to construct

a “maximally fractional” defect, which is automatically SN invariant2. In a twisted sector

corresponding to a single w cycle, the doubled boundary state is given by

| Ba⟩⟩(w) =
∑︂
i

Sai
S0i

∑︂
n

|i, n⟩(1)(w) ⊗ |i, n⟩
(2)

(w)

∑︂
m

|i,m⟩(2)(w) ⊗ |i,m⟩
(1)

(w) , (3.5.1)

where the sum over n,m denotes the sum over all the descendants (including fractional

Virasoro modes) of the w-twisted sector primary |i⟩(w). Using these boundary states for

single cycles, we can construct a defect boundary state which is labeled by the representation

R of SN as well as the choice of primary a of the RCFT as

| BR
a ⟩⟩ =

∑︂
[g]∈SN

χR([g])
N∏︂
j=1

lj∏︂
kj=1

| Ba⟩⟩(j) . (3.5.2)

The consistency condition for the topological defects derived by Petkova and Zuber in [115]

is equivalent to the Cardy condition for the doubled boundary state (3.5.2). The cylinder

amplitude for two defect-boundary states is given by

ZR1R2
ab (q) = ⟨⟨BR1

a | qL
(1)
0 +L̄

(1)
0 − c

12 qL
(2)
0 +L̄

(2)
0 − c

12 | BR2
b ⟩⟩

=
∑︂

[g]∈SN

χ̄R1([g]) χR2([g])
N∏︂
j=1

(︄∑︂
i

S∗
ai

S0i

Sbi
S0i

χi(t/j) χi(t/j)

)︄lj

. (3.5.3)

The Cardy condition states that under modular transformation to the annulus channel, the

partition function has a consistent interpretation as an open string partition function, i.e.

the primary representations appear with integer multiplicities. Using the modular transfor-

mation of the RCFT characters and the Verlinde formula, one obtains

ZR1R2
ab (q̃) =

∑︂
[g]∈SN

χ̄R1([g]) χR2([g])
N∏︂
j=1

(︂∑︂
rs

N rs
ab χr(jt̃) χs(jt̃)

)︂lj
, (3.5.4)

2For discussions on a more general construction of D-branes in symmetric orbifold CFTs see [145].
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where N rs
ab can be expressed in terms of the fusion coefficients nabc of the seed RCFT

N rs
ab =

∑︂
i,k,j

S∗
aiSbiSik
S0i

S∗
kjSjrSis

S0j

=
∑︂
k

nkab n
rs
k . (3.5.5)

Consequently, the N rs
ab are non-negative integers. The partition function appearing in (3.5.4)

Zab(t̃) =
∑︂
rs

N rs
ab χr(t̃) χs(t̃) , (3.5.6)

contains the characters of the folded RCFT with integer multiplicities and can be written

as a trace over a Hilbert space Hab in the doubled tensor product of the seed RCFT. Hence,

(3.5.4) can be written as

ZR1R2
ab (q̃) =

∑︂
[g]∈SN

χ̄R1([g]) χR2([g]) tr(Hab)⊗N

(︂
g q̃L0− c

24

)︁
, (3.5.7)

and the character sum projects onto the representations of SN in the N -fold tensor product

of the folded CFT of R1 and R2. It follows that the open string partition function will be

a sum over states with integer multiplicity. The maximal fractional boundary state (3.5.1)

satisfies the Cardy condition and, therefore, defines a consistent topological defect.

It follows from unfolding the boundary state (3.5.2) that the quantum dimension of the

maximally fractional defect Ia,R labelled by a,R is given by

⟨Ia,R⟩ = ⟨0 | BR
a ⟩⟩ = χR([1])

(︃
Sa0
S00

)︃N
, (3.5.8)

which is the product of the quantum dimension of the universal defect and the quantum

dimensions of the N copies of the topological defect in the RCFT present in the untwisted

sector. Similar considerations as presented above determine the fusion coefficients of the

defects as well as their defect Hilbert spaces.

The construction of the maximally fractional defects can straightforwardly be extended to

other seed CFTs including compact bosons, T 4, andK3 sigma models (see e.g. [118, 136, 146–

150]), where the RCFT defects in (3.5.2) are replaced by topological defects of the seed CFT,

which realize more general non-invertible symmetries. We leave the discussion of these defects

for future work.
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3.6 Large-N symmetric orbifold

In this section, we discuss the universal defects of section 3.3 in the large-N limit. We

provide a criterion for a defect to be non-trivial in this limit. Then, we show that there

exist representations that pass this criterion. In the next section, we will argue that in the

AdS3/CFT2 correspondence, these non-trivial defects correspond to topological defects on

the worldsheet.

σ[g]

IR

= χR([g])
dimR

σ[g]

IR

+
∑︁
R′ ̸=⊮

∑︁
i,v

ciRR′([g]) v σR
′,i

[g]

IR
IR′

Figure 3.9: Action of the topological defect IR on twist operators. The vector v is an element

in Hom(R ⊗ R,R′). The sum on the right-hand side is over R′ with NRR
R′ ̸= 0 . We have

omitted the orientation of the defect since all the representations of SN are real.

Consider the topological defect IR, the general action on twist operators is shown in

Figure 3.9. This depends on the Kronecker coefficients NRR
R′ as well the constants ciRR′([g]).

The former determines the representations R′ that appear in the sum. In principle, to

determine the constants ciRR′([g]) we need to know both the Kronecker coefficients as well as

the F-symbols. At present, it is an open problem in mathematics to find explicit expressions

for the Kronecker coefficients for arbitrary representations. In fact, it is known that the

Kronecker coefficients in general are unbounded for large-N [151].

For a defect to be non-trivial in the large-N limit, it needs to satisfy3

lim
N→∞

χR([g])

dimR

< 1 . (3.6.1)

If this is not the case, in the limit N → ∞ the defect commutes with all the operators and

therefore the contributions of non-local operators are zero (see section 2.2.4 of [14]). We

conclude that for finite N the contributions of non-local operators on the right-hand side of

Figure 3.9 are subleading.

3Note the characters satisfy χR([g]) ≤ dimR for any representation.
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Let us now comment on what representations lead to non-trivial Ward identities in the

large-N limit. Recall that as is the case for the conjugacy classes, representations of SN are

also labeled by partitions of N 4

R : (r1, r2, . . . ), r1 + r2 + · · · = N . (3.6.2)

We can associate a Young tableau to each representation where the number of boxes in the

row i is equal to ri. For a representation R,5 the character of a conjugacy class with a single

cycle has the following limit [152, 153]

lim
N→∞

χR([n])

dimR

=
∑︂
i

αni − (−1)n
∑︂
i

βni , (3.6.3)

where αi = lim
N→∞

ri
N

is the number of boxes in row i divided by N . Similarly, βi is the

number of boxes in the column i divided by N . As an example, let us look at the standard

representation of SN , which corresponds to the Young tableau

· · ·

with the corresponding partition being (N − 1, 1). We see that

α = lim
N→∞

(︃
N − 1

N
,
1

N
, 0, 0, . . .

)︃
= (1, 0, 0, . . . ) , (3.6.4)

and

β = lim
N→∞

(︃
2

N
,
1

N
,
1

N
. . .

)︃
= (0, 0, 0, . . . ) . (3.6.5)

Hence, in the large-N limit χS([g])
dimS

→ 1. This can also be derived by calculating the character

of the standard representation for finite N using the Frobenius formula. Therefore, we

4Here we are using a different notation to label partitions of N compared to section 3.3 where li is the
number of ri’s that satisfy ri = i.

5The representation needs to have a well-defined limit, see for example [152].
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conclude that the Ward identities of the standard representations are trivial in the large-N

limit and only constrain subleading contributions coming from higher genus covering spaces.

Examples of representations with nontrivial ratio χR([g])
dimR

in the large-N -limit are Young

diagrams with two rows and diagrams of hook-shape. For both of the above, the Kronecker

coefficients NRR
R′ are known [154–156]. For example, for the Young diagram with two rows

· · ·

· · ·

we have

α =

(︃
1

2
,
1

2
, 0, . . .

)︃
, β = (0, 0, 0, . . . ) , (3.6.6)

and therefore
χR([n])

dimR

→ 1

2n−1
. (3.6.7)

Thus, we expect the defect corresponding to this representation to be non-trivial in the

large-N limit.

3.7 Non-invertible symmetries and AdS3/CFT2 duality

The tensionless limit of the type II AdS3 × S3 × M4 background with NS-NS flux is a

holographic setup where the non-invertible symmetries of the SN orbifold CFT are realized.

In this section, we take some first steps in constructing the holographic duals of these defects
6.

3.7.1 Tensionless Limit

In recent years, an example of an exact AdS/CFT duality has been established, relating type

II string theory on AdS3×S3×M4 with k = 1 units of NS-NS flux to the symmetric orbifold

CFT M⊗N
4 /SN in the large-N limit. Here, M4 is the CFT defined by the supersymmetric

6See the recent paper [157] for related discussions.
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sigma-model with target space T 4 or K3. The characteristic feature of this duality is that

the string theory is defined on highly curved spaces far away from the supergravity limit,

yet a tractable worldsheet CFT exists. The worldsheet description is based on a product of

a PSU(1, 1|2) WZW model times a twisted M4 sigma model [19, 158]. The agreement of

the spectra on the AdS and CFT side was demonstrated in [19, 20], correlation functions

were identified in [141, 159], the torus partition function was related to thermal AdS in [160],

and D-branes on both sides were related in [144]. The identification of states on both sides

relates the vertex operators O(w)
h (x) for a CFT state in a single cycle twisted sector labeled

by w and a seed CFT state labeled by h, to a worldsheet vertex operator V w
h (x; z) where w

now denotes the w-spectral flow sector. This duality relates string amplitudes to the orbifold

worldsheet correlation function

⟨︁
O(w1)
h1

(x1) O(w2)
h2

(x2) · · · O(wn)
hn

(xn)
⟩︁
S2

=

∫︂
Mg,n

dµ
⟨︁
V w1
h1

(x1; z1)V
w2
h2

(x2; z2) · · ·V wn
hn

(xn; zn)
⟩︁
Σg,n

. (3.7.1)

The equality of both sides hinges on a remarkable localization property of the string path

integral. The integral over the moduli space Mg,n only contributes if a holomorphic covering

map exists from the worldsheet Σg,n to the spacetime S2. In this map, the vertex operator

locations zi on the worldsheet are mapped to the locations xi of the CFT operators. These

points have ramification indices wi for i = 1, 2, · · · , n. The covering map behaves like

Γ(z) = xi + aΓi (z − zi)
w
i +O

(︁
(z − zi)

wi+1
)︁
, (3.7.2)

near z = zi and hence close to zi describes a wi-fold cover. The fact that the string worldsheet

path integral localizes was shown using worldsheet Ward identities in [21] (see [161–165] for

further discussions). In the following, we will focus on correlation functions at leading order

in large-N, where both the string worldsheet and the target space are two spheres. This map

allows us to reverse engineer the topological defect on the string worldsheet.

We recall that the topological defect operators associated with Rep(SN) given in (3.3.3)

are projectors on the twisted sectors of the SN orbifold, weighted by the character of the
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representation

ICFT
R =

∑︂
[g]

χR([g])P[g]P̄[g] . (3.7.3)

Single string states created by the vertex operators V w
h (x, z) in the spectral flow sector w

correspond to single cycle twisted states of length w. Limiting ourselves to the single cycle

twisted sector, a natural proposal for a worldsheet is the projector

Iws
R =

∑︂
w

χR([w])PwP̄w , (3.7.4)

where Pw is a projector on the w-spectral flow sector and χR([w]) is the SN character of a

single cycle conjugacy class of length w in representation R.

Such a projector7 can be constructed as an operator on the worldsheet using the free

field Wakimoto construction [171] of the SL(2,R) part of the worldsheet sigma model. As

an initial step, we define I[C] as a contour integral over the worldsheet bosonic field Φ(z)

I[C] = −2

∮︂
C

dz

2πi
∂zΦ , (3.7.5)

where the contour C is always oriented counterclockwise. The localization of the worldsheet

path integral [21, 161, 162], pictorially shown in Figure 3.10, leads to a very special property

of the ∂zΦ(z) field when inserted in string correlation functions [21]

⟨
(︁
− 2∂Φ(z)

)︁
V w1
h1

(x1; z1) · · ·V wn
hn

(xn; zn)
⟩︁
=
∂2zΓ(z)

∂zΓ(z)
⟨V w1

h1
(x1; z1) · · ·V wn

hn
(xn; zn)

⟩︁
. (3.7.6)

The expectation value of I(C) can then be evaluated using the following identity for the

covering map Γ

∂2zΓ(z)

∂zΓ(z)
=

n∑︂
i=1

wi − 1

z − zi
−

N−1∑︂
a=1

2

z − z∗a
. (3.7.7)

Here, za are the location of the “secret poles,” which in general depend on the location of the

CFT operators xi and are necessary for the existence of the covering map. We have placed

7Another proposal for I[C] is the boundary central term I =
∮︁

da
2πi

∂zγ
γ [166–170]. This operator gives the

winding number of the covering map Γ(z), but the winding number is only defined with respect to a base
point (z = 0 in the given formula) and does not lead to a viable worldsheet version of the topological defect.
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the N -th secret pole at z = ∞, which is always possible and doing so cancels the background

charge of Φ at infinity as discussed in [21]. It is easy to verify that the residue of ∂2zΓ/∂zΓ at

infinity is zero using the Riemann-Hurwitz formula. The value of I[C] for a given contour

can now be determined using the residue theorem.

We can now give a proposal for Iws
R [C], i.e. the worldsheet version of the topological

defect for contour C

Iws
R [C] =

∑︂
w

χR(w)δw−I[C]

=
∞∑︂
w=1

χR(w)

∫︂ 2π

0

dα

2π
exp

(︂
iα
(︁
w − 1− I[C]

)︁)︂
. (3.7.8)

Thanks to the localization formula (3.7.6) and (3.7.7), it is easy to see that (3.7.5) evalu-

ates to wi−1 for a countour which encircles only zi and is independent of small deformations

of the contour. Hence, (3.7.8) is acting like the projector (3.7.4) when encircling a single

vertex operator. In particular, if the contour is inserted around a vertex operator in the

untwisted sector (this can be the ground state itself), we have wi = 1 and I[C] evaluates to

zero and hence Iws
R [C] evaluates to χR([1]), i.e. the quantum dimension of the operator.

x1

x4

x3

x2

C

ω1

ω2

ω3

ω4

z1

z2

z3

z4

w
or

ld
sh

ee
tbo
un

da
ry

Figure 3.10: Contour C of operator I enclosing a vertex operator localized at x1.

Consider now a two-point function of twist operators on the boundary. The dual correla-

tor is a two-point function of spectrally flowed vertex operators. It is not too difficult to check

that the value of Iws
R [C] around any of the two insertions is the same. This is consistent with

inserting the corresponding operator ICFTR on the boundary around either operators which
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gives the same value. The more interesting case is when we insert the operator ICFTR around

a line that does not enclose any operator. This gives the dimension of the representation.

On the worldsheet, the corresponding operator Iws
R [C] will be along a curve with no vertex

operator inside giving again the dimension of the representation. However, in this case, the

contour integral in I[C] with no poles inside is not equal to the sum of the contour integrals

around each of the vertex operators. This is because of the the presence of the secret poles

in (3.7.7). On the worldsheet, we interpret this as the result of the lasso effect described in

Figure 3.3.

The sign (alternating) defect is an example of an invertible defect for which χA(w) =

(−1)w+1. When inserted on the boundary, the defect enforces the selection rule that
∑︁

iwi

is odd. Since the character of the sign representation on single cycles of length w satisfies

χA(w + 2) = χA(w), we see that Iws
R [C] is blind to the secret poles (they contribute −2

to the contour integral) and, therefore, the contour integral can be written as a sum of

contour integrals around the ramification points reproducing the correct Ward identity on

the worldsheet. The same line of reasoning can be applied to the case of three-point functions

reproducing the corresponding Ward identities on the worldsheet.

3.7.2 Deformation away from the k = 1 and the supergravity limit

Turning on RR-fluxes in the bulk corresponds to deforming the symmetric orbifold CFT by

an exactly marginal deformation [165, 172–182]. This deformation is proportional to a two-

cycle twist field which we denote by σ[2]. In the following, we argue that this deformation

breaks all the non-invertible universal defects associated with the representations of SN .

Consider the action of a topological defect IR on the twisted state created by σ[2]

IR |σ[2]⟩ = χR([2]) |σ[2]⟩ . (3.7.9)

The deformation breaks all the defects if and only if χR([2]) ̸= dimR. Below we prove that

no defect satisfies this and, therefore, all the universal defects are broken in the supergravity

limit.
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Consider an element g in some representation R. Since all finite groups are unitariazable,

this is a dimR × dimR matrix whose eigenvalues satisfy |λi| = 1. Hence,

χR(g) =

dimR∑︂
i=1

λi , |λi| = 1 . (3.7.10)

We see that χR(g) = dimR if and only if λi = 1 ∀ i which is true only for the trivial

representation. Hence, we conclude that any marginal deformation involving twist operators

breaks all the universal defects. This means that all nontrivial symmetries do not survive

the deformation away from the k = 1 point.

3.8 Entanglement Entropy and Topological Defects

In this section, we calculate the entanglement entropy for topological defects in symmetric

orbifold CFTs using the methods developed for topological defects in rational CFTs in [5,

183, 184]. The defect entropy we calculate can be viewed as a measure of the complexity

of the defect. Furthermore, it provides an observable which may be of use in calculating

the entanglement entropy holographically using the dual AdS3 × S4 ×M4 background with

the minimal k = 1 unit of NS-fivebrane flux [18–21, 127]. Such a calculation may provide a

further check on the proposals of the dual of the topological defect operators put forward in

[6, 185].

3.8.1 Entanglement entropy and topological defects

In two dimensional CFTs, the simplest example of entanglement entropy is given by consid-

ering the theory in its vacuum and a single spatial interval A. The entanglement entropy

is then given by the von Neumann entropy of the reduced density matrix ρA = trĀ |0⟩⟨0|,

where we trace over the states in the complement of A.

SA = − tr ρA ln ρA . (3.8.1)
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The replica trick allows the entanglement entropy to be calculated from Rényi entropies

SA = −∂K tr ρKA

⃓⃓⃓
K=1

. (3.8.2)

The K-th Rényi entropy can be calculated by a path integral over a Riemann surface with K

sheets, with branch cuts along the interval A connecting the sheets in a cyclic fashion. The

entanglement entropy for the CFT in its ground state can be obtained from the partition

function Z(K) over the K-sheeted Riemann surface, by the following expression

SA =
(︁
1− ∂K

)︁
lnZ(K)

⃓⃓⃓
K=1

. (3.8.3)

In the evaluation of the path integral one has to introduce an ultraviolet cutoff ϵ and the

terms which survive the limit of the cutoff going to zero are

SA =
c

3
ln
L

ϵ
+ ln gA , (3.8.4)

where c is the central charge of the CFT. The constant term is not universal in the case

of the CFT defined on a real line in the ground state. However, it can become physical in

the the presence of a boundary or interface [186–188] and is sometimes called the g-factor

or boundary entropy [189]. In the following we would like to calculate this g-factor for

topological defects in symmetric orbifold CFTs.

3.8.1.1 Entanglement of symmetric defect

The g-factor (3.8.4) also appears in boundary CFTs, where the partition function of a CFT

is defined on an interval of length L, with boundary conditions labeled by a and b at the two

ends of the interval.

lnZ = ln tr e−βHab ∼ ln(gagb) +
cπ

6

L

β
+ · · · , (3.8.5)

which is valid in the limit L >> β. After a modular transformation from the open string an-

nulus, the partition function can be viewed as a closed string cylinder between two boundary

states

Z = ⟨⟨a|e−LHcl |b⟩⟩ . (3.8.6)
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One can extract the g-factors by inserting the ground state and taking the L→ ∞ limit. It

follows that

ga = ⟨0|a⟩⟩ . (3.8.7)

It has been shown [187] that for an entangling surface A which starts at the boundary,

the g-factor appearing in the entanglement entropy (3.8.4) is given by (3.8.7). So far we

have considered a boundary CFT. For a conformal interface, one can use the folding trick

[131, 132] where an interface between CFT1 and CFT2 is turned into a boundary CFT by

folding CFT1 × CFT2, which can be represented by a boundary state |B⟩⟩. It was argued

in [187, 188] that the g-factor for the entanglement entropy for a conformal defect which is

symmetric (i.e. in the middle of the entangling region A) is given by (3.8.7), where | a⟩⟩ is

the boundary state representing the defect in the folded CFT.

3.8.1.2 Entanglement entropy of defects at the entangling surface

In order to describe the defect located at the boundary of the entangling region A and its

complement (see the left-hand side of Figure 3.11), we can introduce the K sheeted covering

map with z = lnw. We introduce a UV cutoff ϵ at the boundary of A and an IR cutoff

Figure 3.11: Conformal map for the replicated worldsheet for defects at the entangling

surface, figure from [5].

L as the length of the branch cut. In general, we have to impose boundary conditions at
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the cutoff surfaces with the simplest one being to identify the cutoff surfaces periodically,

which produces a toroidal worldsheet8. It is possible to place a conformal interface at the

boundary, which in the replicated surface will turn into K copies of I and K copies of the

conjugate defect I† placed equidistant on the torus

Z(K) = tr
[︂(︁
Ie−tHI†e−tH

)︁K]︂
. (3.8.8)

The Euclidean time t can be expressed as

t =
2π2

lnL/ϵ
, (3.8.9)

the simplest choice ϵ = 1/L is made in [183] and the limit ϵ → 0 corresponds to removing

the UV cutoff as well as taking L to be large. For conformal defects, the replica partition

function has only been calculated for simple cases such as free bosons and fermions as well

as minimal models [183, 193–195]. In all examples, the entanglement entropy behaves as

follows9

SA =
ceff
6

ln
L

ϵ
+ ln gA , (3.8.10)

where in general ceff is not the central charge c of the bulk CFT but instead depends, in a

complicated fashion, on the details of the conformal interface (see [197] for a recent discussion

on universal properties of ceff).

For topological defects, the expression (3.8.8) simplifies since the defects commute with

the Hamiltonian and they can be combined

Z(K) = tr
[︂(︁
II†)︁Ke−2tKH

]︂
. (3.8.11)

The entanglement entropy derived from this partition function has the form (3.8.10) with

ceff = c. Hence, the leading term in the entanglement entropy does not depend on the

8More general conformal boundary conditions have been considered in constructions of symmetry resolved
entanglement entropy in [186, 190–192].

9The ceff/6 differs from (3.8.4) by a factor of 1/2, this is caused by taking the limit L → ∞ and only
taking the entanglement of one side of the entangling surface into account, see [196] for a discussion on this
issue.
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defect and all information is in the sub-leading g-factor which contains information about

the ground state degeneracy of the interface. It is the goal of the present section to calculate

this quantity for the topological defects in symmetric orbifolds constructed in [6].

3.8.2 Entanglement entropy with symmetric orbifold defect

In this section, we will use the formulas reviewed in subsection 3.8.1 to calculate the entan-

glement entropy in the presence of the topological defects.

3.8.2.1 Universal defects

Using the folded boundary state (3.3.1), it follows from (3.8.7) that the sub-leading contri-

bution to the entanglement entropy for a symmetrically placed topological defect is given

by the logarithm of the g-factor, which in turn is calculated by the overlap of the boundary

state with the vacuum

gA = ⟨0 | BR⟩⟩ = χR(1) = dim(R) . (3.8.12)

Note that gA is given by the quantum dimension of the defect, which is simply the dimension

of the irreducible representation R. For conformal defects, this result is only valid for the

symmetrically placed defect. For topological defects, we can move them away from the

middle and the result will not change unless we come very close to the boundary of the

entangling region.

Note, however, that this is not true for the topological defect at the boundary of the

entangling surface as discussed in subsection 3.8.1. For the universal topological defects, one

finds

Z(K) = tr
[︂
I2Ke−2KtH

]︁
=
∑︂
[g]

[︁
χR([g])

]︁2K
tr
(︁
P[g]P̄[g]e

−2KtH
)︁
, (3.8.13)

where we used the reality of the characters which implies that I† = I. The modular param-
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eter is given by

τ = i
2πK

ln L
ϵ

. (3.8.14)

The partition function can be expressed as a sum over twisted sectors

Z(K) =
1

|G|
∑︂
hg=gh

[︁
χR([g])

]︁2K
h
g
(τ, τ̄) . (3.8.15)

We can view this as a summation over twisted sectors labeled by g and a projection on SN

invariant states implemented by h, where h runs over the centralizer of g, i.e. all elements

which commute with g. Taking the cutoff L→ ∞ implies that τ → 0, so we have to perform

a modular transformation of the torus partition function

Z(K) =
1

|G|
∑︂
g

∑︂
h∈C[g]

[︁
χR([g])

]︁2K
g−1

h

(−1

τ
,−1

τ̄
) . (3.8.16)

Note that the limit τ → 0 implies that the argument of the modular transformed partition

function behaves as − 1
τ
→ ∞. Hence, the partition function is dominated by the sector

with the primary of the lowest conformal dimension. For the symmetric orbifold, this is the

untwisted vacuum sector.

Note that in the centralizer C[g] of any element g ∈ SN , the identity is always present

since it trivially commutes with any element. Hence, the partition function in the τ → 0

limit is dominated by the untwisted sector

lim
τ→0

Z(K) ∼ lim
τ→0

∑︂
g∈SN

1

|G|
[︁
χR([g])

]︁2K
g

1

(−1

τ
,−1

τ̄
) , (3.8.17)

where we also used the reality of the character to replace g−1 by g in the torus partition

function. In the limit τ → 0 each term in the partition function contributes the same leading

term, which is independent of g.

lim
τ→0

g

1

(−1

τ
,−1

τ̄
) = e−

2πi
τ

(− c
24

)e
2πi
τ̄

(− c
24

) + · · ·

= exp
(︂ c
12

1

K
ln
L

ϵ

)︂{︂
1 +O(e−

1
K

ln L
ϵ )
}︂
, (3.8.18)
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where the central charge is c = Ncseed.

The argument for this is as follows: the modular invariant partition function of the

seed theory is Z(τ, τ̄). Consider an element g ∈ SN which is given by k cycles of lengths

n1, n2, · · ·nk with
∑︁

k nk = N . In the tensor product theory, the partition function with g

inserted is

g

1

(−1

τ
,−1

τ̄
) =

k∏︂
i=1

Zseed(−ni
1

τ
,−ni

1

τ̄
) . (3.8.19)

In the limit τ → 0 the partition function of the seed theory is dominated by the vacuum

contribution

lim
τ→0

g

1

(−1

τ
,−1

τ̄
) ∼

k∏︂
i=1

e−
2πi
τ
nicseed/24e

2πi
τ̄
nicseed/24

∼ e−
2πi
τ
Ncseed/24e

2πi
τ̄
Ncseed/24

∼ exp
(︂ c
12

1

K
ln
L

ϵ

)︂
, (3.8.20)

where we used
∑︁

i ni = N . Putting these ingredients together we obtain

lim
τ→0

lnZ(K) =
c

12

1

K
ln
L

ϵ
+ ln

(︂∑︂
g∈σ

1

|G|
[︁
χR([g])

]︁2K)︂
. (3.8.21)

Consequently, the entanglement entropy in the limit where L is very large can be calculated

using (3.8.3) and one obtains

SA =
c

6
ln
L

ϵ
+ (1− ∂K) ln

(︂∑︂
g∈G

1

|G|
[︁
χR([g])

]︁2K)︂ |K=1 . (3.8.22)

This expression can be simplified using the orthogonality formula of characters and the fact

that characters of SN are real

1

|G|
∑︂
g

χR([g])
∗χS([g]) = δRS . (3.8.23)

We arrive at the final expression for the entanglement entropy of a topological defect at the

entangling surface.

SA =
c

6
ln
L

ϵ
−
∑︂
g

1

|G|
[︁
χR([g])

]︁2
ln
(︂
[χR([g])]

2
)︂
. (3.8.24)
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Note that the expression for the g-factor is considerably more complicated than the sym-

metric one (3.8.12) which is not surprising since most of the entanglement is localized close

to the boundary of the entangling surface.

(a) Defect entropy ln gA for N = 25. (b) ln gA sorted by magnitude for N = 25

Figure 3.12: Universal defect entropy for the irreducible representations of S25.

We can evaluate the defect entropy from the character table of SN and the number of

elements in each conjugacy class, which can be calculated using the GAP software package

[198] for large values of N . In Figure 3.12 we present the results for two cases of N = 25 for

which there are 1958 irreducible representations. In the plot on the left the representations

are dominance ordered, i.e. for two partitions λ, µ of N , one has λ ⊵ µ if λ1+λ2+ · · ·+λi ≥

µ1 + µ2 + · · · + µi for all i. In addition, we give the Young diagram associated with the

representation which has the largest absolute value of ln gA. In the plot on the right, we plot

ln gA in order of magnitude. In Figure 3.13 we present the same plots for N = 35, for which

there are 14883 irreducible representations.

We can recognize a Z2 symmetry in these plots due to the fact that in general a new

irreducible representation can be obtained from an irreducible representation by acting with

the one-dimensional alternating representation. The characters of these two representations

differ only by signs. Since the characters in the formula (3.8.24) appear squared, we get the

same gA for both representations.

We can obtain a bound on the defect entropy ln gA given in (3.8.24) using the fact that
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(a) Defect entropy ln gA for N = 35. (b) ln gA sorted by magnitude for N = 35

Figure 3.13: Universal defect entropy for the irreducible representations of S35.

χR(g) ≤ χR(1) for all g ∈ SN∑︂
g

1

|G|
[︁
χR([g])

]︁2
ln
(︂
[χR([g])]

2
)︂
≤
∑︂
g

1

|G|
[︁
χR([g])

]︁2
ln
(︂
[χR(1)]

2
)︂

≤ 2 ln
(︂
dim(R)

)︂
, (3.8.25)

where we used character orthogonality (3.8.23) as well as χR(1) = dim(R). In [199] an

asymptotic bound for the dimension of the representation dim(R) was derived

ln
(︂
dim(R)

)︂
≤ N lnN −N − c

√
N , (3.8.26)

where c is a constant c ∼ 2.5651. This result bounds the absolute value of the defect entropy.

Numerical evaluation for N ≤ 35 seems to indicate that this bound is not very strong and

it is an interesting question whether a stronger bound exists, but we have not been able to

find one in the mathematics literature.

3.8.2.2 Non-universal defects

For the non-universal defect, the defect symmetric entropy is given by taking the logarithm

of the g-factor for the folded boundary state (3.5.2)

gR,a = ⟨0 | BR
a ⟩⟩ = χR(1)

(︃
Sa0
S00

)︃N
, (3.8.27)
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which follows from the fact that in the untwisted sector we have N copies of the RCFT

defect.

For the calculation of the entanglement entropy at the defect, we have to evaluate the

replicated partition function (3.8.11) with the defect I which is obtained from unfolding the

folded boundary state (3.5.1). Writing down the complete partition function is somewhat

cumbersome due to the summation over the centralizer of g, but we should note that following

the same strategy for calculating the entanglement as in subsection 3.8.2.1 still applies and

the leading contribution is obtained from the partition function in the h = 1 sector, before

modular transformation, which gets mapped to the dominant untwisted sector after modular

transformation

Z(K) =
∑︂
g

1

|G|
(︁
χR([g])

)︁2K N∏︂
j=1

(︄∑︂
i

⃓⃓⃓⃓
Sai
S0i

⃓⃓⃓⃓2K
χi(

τ

j
)χ̄i(

τ̄

j
)

)︄lj

+ · · · . (3.8.28)

The limit τ → 0 of Z is evaluated by an S-modular transformation using the transformation

of the RCFT characters given in section 3.2.1.

lim
τ→0

Z(K) ∼ lim
τ→0

∑︂
g

1

|G|
(︁
χR([g])

)︁2K N∏︂
j=1

⎛⎝∑︂
i,k,k̄

⃓⃓⃓⃓
Sai
S0i

⃓⃓⃓⃓2K
Sik S

∗
ik̄ χk(−j

1

τ
)χ̄k̄(−j

1

τ̄
)

⎞⎠lj

+ · · · .

(3.8.29)

The dominant contribution in the τ → 0 limit in (3.8.29) comes from the vacuum character

χ0, which behaves like q−
cseed
24 q̄−

cseed
24 as q → 0. Using this expansion, and the fact that∑︁

i lj = N for all permutations g ∈ SN , one obtains

lim
τ→0

Z(K) ∼
∑︂
g

1

|G|
(︁
χR([g])

)︁2K(︂∑︂
i

|Sai|2K |S0i|2−2K
)︂N

exp
(︁ c
12

1

K
ln
L

ϵ

)︁
+ · · · . (3.8.30)

Taking the logarithm produces three terms

lim
τ→0

lnZ(K) =
c

12

1

K
ln
L

ϵ
+ ln

(︂∑︂
g∈σ

1

|G|
[︁
χR([g])

]︁2K)︂
+N ln

(︂∑︂
i

|Sai|2K |S0i|2−2K
)︂
+ · · · .

(3.8.31)

Consequently, the entanglement entropy in the limit where L is very large can be calculated
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using (3.8.3) and one obtains

SA =
c

6
ln
L

ϵ
−
∑︂
g

1

|G|
[︁
χR([g])

]︁2
ln
(︂
[χR([g])]

2
)︂
−N

∑︂
i

|Sai|2 ln

(︄⃓⃓⃓⃓
Sai
S0i

⃓⃓⃓⃓2)︄
, (3.8.32)

where we have repeated the calculation of subsection 3.8.2.1 to obtain the second term and

used the unitarity and symmetry of the modular S matrix, in particular
∑︁

j |Saj|2 = 1 as

in [5, 184]. It is interesting that for the “maximally fractional" universal defect, the defect

entropy ln gA is the sum of the contribution of the universal defect (3.8.24) and N times the

contribution of the RCFT topological defect [5, 184]. This together with the result for the

symmetric entanglement entropy (3.8.27) indicates that the maximally fractional defect can

be in some sense viewed as a product of the RCFT and symmetric orbifold defect.

3.9 Discussion

In this work, we investigated certain aspects of the universal topological defects of the sym-

metric orbifold CFT M⊗N/SN . These defects are universal in the sense that they do not

depend on the details of the seed CFT, and exist in any SN orbifold theory. Using modu-

lar transformations of torus partition function, we determined universal defect operators on

which the topological lines can end. These operators are built on the twisted sector ground

states. These states are derived from the vacuum of the seed CFT and hence do not depend

on the details of the seed CFT other than the central charge and the conjugacy class labeling

the twisted sector.

The non-invertibility of the symmetry leads to Ward identities which relate correlation

functions of local operators to (sums of) correlation functions of defect and local operators

with lines as well as junctions inserted. We illustrated this in the simplest example which

exhibits non-ivertible symmetries, namely the S3 symmetric orbifold.

In addition, we constructed an example of a non-universal defect which is built from a

topological defect in the seed CFT (which we took to be diagonal RCFTs with Verlinde lines).

This “maximally” fractional defect satisfies the Cardy constraints and it would be interesting

to see whether more general solutions (maybe along the lines of similar constructions for
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D-branes in symmetric orbifolds in [145]) are possible. The maximally fractional defect we

constructed in the present paper can be, in some sense, viewed as a product of the RCFT

and symmetric orbifold defects.

We provided a criterion that determined which universal defects are non-trivial in the

large-N limit. This was possible due to the known asymptotic behavior of SN characters. It

would be particularly interesting to study the Ward identities of non-trivial defects in the

large-N limit. At this moment, this task looks daunting since there are no explicit expressions

for both the F-symbols as well as the Kronecker coefficients of SN to our knowledge.

The universal defects of the orbifold CFT are interesting in the context of AdS3/CFT2

correspondence. We argued that these defects correspond to defects on the worldsheet, a case

distinct from previous examples where boundary topological defects correspond to D-branes

in the bulk. This is a peculiarity of the tensionless limit. This idea has appeared recently

in other works [157, 200]. On the boundary, passing an operator though a topological defect

generally produces non-local operators. It would be interesting to understand the holographic

dual of these operators.

Away from the orbifold point, we showed that the universal defects are broken explicitly

by a marginal deformation. Hence, these defects do not generally exist in the supergravity

limit. It would be interesting to understand what happens when the deformation parameter

is infinitesimal and what role these softly broken defects might play in holography.

In this work, we focused on the tensionless limit with k = 1. This corresponds to the

smallest possible radius for AdS3. For higher values of k, it is believed that the boundary

theory is tensored with a Liouville factor but remains an orbifold CFT [170]. Hence, we

expect our universal defects to be present for higher values of k as well. It would be interesting

to understand the holographic dual of the universal defects in the large k limit where semi-

classical supergravity computations are more reliable.

We also calculated the entanglement entropy of a single interval in the presence of uni-

versal and non-universal topological defects. For symmetric placement, the defect entropy is

the logarithm of the quantum dimension. For a defect at the entangling surface, it depends
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on the characters of SN and, for non-universal defects, on the modular S matrix of the seed

RCFT. We evaluated the universal defect entropy numerically for N ≤ 35.
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CHAPTER 4

Quantum Field Theory in Non-Integer Dimensions

4.1 Introduction and summary

The goal. Chiral gauge theories are famously difficult to analytically continue away from

integer dimensions, an obstacle first raised in the context of dimensional regularization [201–

203]. There, the motivation for extending d ∈ N to d ∈ C was that such a continuation

is an extremely convenient regulator, massively simplifying computations. For vector-like

theories, this continuation was promptly solved, but chiral theories, which involve the matrix

γ⋆, required significant extra work. Arguably, a completely satisfactory treatment, especially

in the context of supersymmetric theories [204, 205], is still lacking. That being said, various

working prescriptions are known: for example, one can use the standard ’t Hooft-Veltman

trick, where we split our spacetime into two submanifolds, the “transverse” and “parallel”

directions, and define γ⋆ only with respect to the latter. For instance, if we were working in

d = 2 + ϵ, we would typically declare that

{γ⋆, γµ} = 0 µ = 1, 2

[γ⋆, γµ] = 0 µ ̸= 1, 2 (4.1.1)

This is all well and good if we are interested in eventually taking d→ 2, but not otherwise:

if we use this continuation in d, and take d→ 4 instead, the answer we would get would differ

from the correct one as computed directly in d = 4. In other words, ’t Hooft-Veltman-like

prescriptions are only useful for an infinitesimal neighborhood around a given d ∈ N.

Here we are more ambitious and would like to extend various theories to a non-
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infinitesimal subset of the complex d plane, in the sense that we want a family of QFTs,

labeled by d ∈ C, which exactly matches the corresponding QFT when we take several

distinct d ∈ N. In other words, a small patch around some specific d ∈ N is not enough for

us: we want some open set in C that contains at least a couple of distinct integer dimensions

d, with agreement when restricted to those. ’t Hooft-Veltman-like prescriptions like the one

above are insufficient for this.

Motivation. There are various motivations for this endeavor. First, a better understand-

ing of this continuation for generic d instead of d close to some specified integer might

help us in coming up with better prescriptions for dim-reg, perhaps eventually leading to a

completely satisfactory treatment of SUSY theories.

But, beyond practical reasons like dim-reg, a proper continuation of QFT to fractional

d has attracted significant attention in recent years, see e.g. [206–229] for a very incomplete

list of examples. Before we try to define this continuation more precisely, let us spend a few

paragraphs explaining some of the reasons why this operation is interesting in the first place.

For us, the fundamental reason is structural: analytic continuation of discrete parameters

allows us to meaningfully connect different QFTs in the space of theories. For example, we

intuitively tend to think of 2d Ising and 3d Ising as “the same theory”, just at different values

of d. On the other hand, one would never say that 2d Ising is the same theory as, say,

3d ABJM. The reason the former QFTs are “the same” but the latter are not is that the

parameter d in Ising can be continued to d ∈ C, and observables become analytic functions of

this variable1. This is the same reason we think of the O(N) model as “the same theory”, just

at different values of N : this makes sense only because the parameter N can be analytically

continued2. This is not just a question of academic interest, but has important practical

implications:

• The ϵ expansion [239] explicitly assumes that the d = 3 and d = 4 theories are con-

1Throughout this paper we will use “analytic” to actually mean “meromorphic”.

2See e.g. [230–238] for some recent literature on analytic continuation of N .
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nected in the space of QFTs. The fact that this technique works at all relies on analytic

continuation in d. Indeed, unless there is “something” in between Ising4 and Ising3,

this expansion would be entirely meaningless. For example, one would never expect to

be able to solve graphene by expanding, say, Banks-Zaks around d = 4.

• The large N expansion explicitly assumes that the O(N) theory and the O(N + 1)

theory are connected in the space of QFTs. As before, one would never expect a 1/N

expansion to work for a random sequence of QFTs, say, something like T (1) = Ising,

T (2) = SU(2) + ψadj, T (3) = abelian Higgs, etc. This expansion works for O(N), but

not for T (N), precisely because the former make up a sequence that is analytic in N .

The goal of the analytic continuation program is to make this intuition rigorous: in

what precise sense are these theories connected to each other in the space of QFTs? Is this

continuation unique? And what does the interpolation teach us about the individual QFTs?

Another common motivation is that analytic continuation in d leads to controlled viola-

tions of unitarity [240], making them a very nice playground for studying non-unitary QFT.

For instance, [241] examines the free energy in QED in continuous dimension in order to

scrutinize the F -theorem [242, 243], which in principle is only proven to hold in unitary the-

ories [244]. More generally, the fundamental principles of the conformal bootstrap program

are rather agnostic to the concrete value of d, and the formalism itself appears particularly

well adapted to treating this integer as a continuous parameter [245].

Yet another reason it is worth our while to explore this continuation is that much of

the emergent phenomena in QCD-like theories that we usually care about, such as non-

perturbative symmetry breaking, infrared dualities, confinement, etc., are present in many

examples in different integer dimensions [12, 13, 246–279]. If we were able to extend these

theories to fractional d, we could try to track these phenomena as we go from one integer

dimension to another, which would likely teach us quite a bit about the concrete mechanisms

behind these features in our original, integer-dimensional gauge theories.

As a concrete example, there are in the literature various instances of gauge theories that
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confine in d = 4 (see e.g. [280]), but deconfine in d = 3 (see e.g. [281, 282]). In this case, one

could guess that there is a confinement/deconfinement transition at some d⋆ ∈ [3, 4], which

could shed some light on the dynamics of the analogous transition in real-world QCD.

A related example is the fact that the critical number of flavors for which there is sym-

metry breaking, N⋆
f , is meaningful in both d = 3 and d = 4, but in principle these two

numbers are independent [283]. By extending QCD to fractional d we get an interpolation

between N⋆
f (d = 4) and N⋆

f (d = 3), potentially connecting these two quantities. With some

wishful thinking, it might be possible that connecting these two objects could lead to a better

understanding of both3.

So, with these motivations in mind, here we reconsider the problem of extending a given

QFT to d ∈ C. As mentioned above, this problem is particularly tricky for chiral theories

but, at least naively, one would expect that vector-like theories can be continued without

significant complications. In this work we point out that, already for vector-like theories,

this continuation is very subtle and, despite what some partial results might suggest, still an

open problem.

Complications. In section 4.2 we will discuss much more carefully the various options for

how this analytic continuation is defined in the first place. For the purposes of this summary,

let us settle for a vague, aspirational prescription: compute things for general d ∈ N and, if

the answer is “uniform in d”, declare that the result is also true when d ∈ C.

The main obstruction to naive prescriptions like the one above is the existence of low-

rank exceptions : situations where observables are not in fact “uniform in d”. The simplest

example where this shows up is the free, massless Dirac fermion. Consider the scalar ψ̄ψ;

its first few correlation functions are all unremarkable: for example, the two-point function

equals ⟨ψ̄ψ(x)ψ̄ψ(0)⟩ ∝ 1/x2(d−1). This result has an obvious continuation to d ∈ C.

The three- and four-point functions of ψ̄ψ are also both uniform in d, but something

interesting happens for the five-point function. By brute-force computation one can check

3As a simple example, [284] used the known value N⋆
f (d = 2) = ∞ to improve their estimate of N⋆

f (d = 3).
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that it vanishes for all integers d ≥ 4, but it is non-zero in three dimensions:

⟨ψ̄ψ(x1) · · · ψ̄ψ(x5)⟩ ∝ δ3,d (4.1.2)

(see (4.2.12) for the actual d = 3 expression). What should its continuation to d ∈ C be?

The answer is far from obvious, at least to us: the integer sequence δ3,d has no canonical

continuation to d ∈ C. (There are infinitely many functions that interpolate this sequence,

but there is no criterion that singles out a specific choice.)

The phenomenon above is in fact quite generic in QFT: most correlation functions have

a qualitative, discrete change in behavior at some finite d ∈ N, which complicates any naive

attempts at making d ∈ C. We next explain the main mechanism for this discontinuity in d.

Consider the n-point function of some scalar operator O(x):

⟨O(x1) · · · O(xn)⟩ (4.1.3)

We assume that our family of QFTs is invariant under translations and rotations, i.e., the

special euclidean group SE(d) = SO(d)⋉Rd. This symmetry then implies that this correlator

is defined on Confn(Rd)/SE(d), i.e., it can be expressed in terms of scalars constructed out

of vi = xi − xi+1.

What are these scalars, specifically? If the number of insertions is small enough, the

ring of SO(d)-invariants is generated by the matrix of inner products gij = vi · vj. But if

the number of vi’s is at least as large as the dimension of Rd, there is one more piece of

SO(d)-invariant information that is not captured by gij, namely the orientation defined by

the basis v1, . . . , vd. In other words, in this case the ring of SO(d)-invariants is generated by

gij together with ε = sign(det(v1, . . . , vd)). Therefore, one can generically write

⟨O(x1) · · · O(xn)⟩ =

⎧⎪⎪⎪⎨⎪⎪⎪⎩
Seven
d,n (gij) + εSodd

d,n (gij) d ≤ n− 1

Seven
d,n (gij) d > n− 1

(4.1.4)

for some functions S (even/odd refer to the intrinsic parity, see below). This is an example

of a small-d exception we mentioned above. For fixed n, there is a discontinuous change
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between d ≤ n − 1 and d > n − 1, which means that the correlation function cannot be

uniform in d: to the extent that there is a meaningful continuation to d ∈ C, there should

be some sort of jump around d ≈ n− 1.

Things are a little nicer if we assume that the theory also has reflection symmetry,

namely that it is invariant under the full euclidean group ISO(d) = O(d)⋉Rd. In this case,

correlation functions of parity-even scalars are defined on Confn(Rd)/ISO(d). Importantly,

ε is parity-odd, and therefore it cannot appear in their correlation functions. In other words,

Confn(Rd)/ISO(d) is coordinatized by the Gram matrix gij alone. In the notation above, the

n-point function equals Seven
d,n (gij) for all d. As there is no fundamental change in behavior

as we vary the number of spacetime dimensions, there is hope that a nice continuation to

d ∈ C might exist.

Parity-odd operators, on the other hand, are less constrained than parity-even ones.

Under a parity transformation, the n-point function picks up the sign (−1)n. Therefore, if n

is even, this forbids the presence of ε, but if n is odd, it forces its presence instead. Therefore,

the case of n even should be uniform in d, but the case of odd n is again discontinuous: the

correlation function must vanish if d > n − 1. This explains why the two-point function

of the parity-odd operator ψ̄ψ was well-defined for d ∈ C, but the five-point function was

∝ δ3,d.

The final conclusion is, then, that generic operators in SO(d)-invariant theories, and

parity-odd operators in O(d)-invariant theories, present discrete, qualitative changes in be-

havior as we vary d ∈ N, and uniform answers only emerge for sufficiently large d. In

the naive approach to analytic continuation, observables become analytic in d only after

we ignore by hand low-rank exceptions. In an intuitive sense, the low d behavior is non-

perturbative in 1/d. Needless to say, at the end of the day we only care about QFTs in low

dimension anyway, which makes the problem both hard and interesting.

Let us mention for completeness that, for more general QFTs where the symmetry group

is neither SO(d) nor O(d), but some more complicated global form of so(d), the question is

whether the representation theory of this global group is stable or not, i.e., whether there
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are low-rank isomorphisms in Rep(G). For example, in the case of G = SO(d) one has the

low-rank isomorphism ∧d[1] ∼= 1, which allows for the exceptional scalar det(v1, . . . , vd). We

will discuss this in more detail in section 4.2.2.

An important incarnation of the subtleties associated with small d exceptions is the fol-

lowing. Say, for example, that we are interested in a perturbative theory defined for general

d, whose spectrum contains a pair of scalar operators O1 and O2. If their scaling dimensions

are different, then these operators cannot mix, and we can compute loop corrections inde-

pendently. But if the scaling dimensions depend on d, and there is some d⋆ for which there

is level crossing, then perturbation theory breaks down around d ≈ d⋆, and we must switch

to degenerate perturbation theory (see e.g. [285, 286]). This typically gives rise to branch

points close to |d| = d⋆. So far, this is standard CFT phenomena.

The striking fact is that this phenomenon can occur even if O1 and O2 have different

spin. For example, a rank-2 anti-symmetric field fµν is different from a vector vµ for generic

d, but the isomorphism [1,1] ∼= [1] in SO(3) means that these two fields have the same

spin in three dimensions, and therefore they can once again mix. Low-d accidental spin

degeneracy is rather common, and our general expectation is that analytically continued

QFTs will develop branch cuts all over the complex d plane.

We can see this explicitly in the main example we will be looking at in this paper: QCD

with gauge group G and fermions ψ in some representation R ∈ Rep(G). We will take the

limit of large R in order to be able to access CFT data reliably.

In section 4.3 we will compute the scaling dimension of the defect operator ψ to leading

order in 1/ dim(R). To tree level ∆(0)(ψ) = (d− 1)/2, and the first correction is

∆(1)(ψ) =
4(d− 1)2Γ(d− 2)

dΓ(d/2)3Γ(1− d/2)

dim(G)

dim(R)
(4.1.5)

This quantity admits a natural continuation in d.

On the other hand, for the scaling dimension of the local operator ψ̄ψ, the first correction

turns out to be

∆(1)(ψ̄ψ) =
4(d− 1)2Γ(d− 2)

dΓ(d/2)3Γ(1− d/2)

(︃
2− d− 4

d− 2

tr[γαµν ] tr[γαµν ]

tr[1]2

)︃
dim(G)

dim(R)
(4.1.6)
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We find the structure tr[γαµν ] tr[γαµν ], which vanishes for all integers d ̸= 3, but is non-zero

for d = 3. Unlike ∆(ψ), this scaling dimension doesn’t have an obvious analytic continuation

in d.

As emphasized above, the obstruction to analyticity in d is the existence of low rank

exceptions, in this case the exception being the 3d isomorphism [1,1,1] ∼= 1, which allows

tr[γµνρ] to be non-zero.

The usual way to recover analyticity in the literature is to declare that tr[γµ1···µn ] ≡ 0 for

all d ∈ C. If we do this, the scaling dimension above becomes

ˆ︁∆(1)(ψ̄ψ) =
8(d− 1)2Γ(d− 2)

dΓ(d/2)3Γ(1− d/2)

dim(G)

dim(R)
(4.1.7)

where the hat signifies that this holds only for generic d ∈ N, but not necessarily for all

d ∈ N. This formula is now analytic in d, and it agrees with ∆(1) for all integers d > 3, but

it gives the wrong answer when d = 3. Therefore, this prescription fails to provide a good

analytic continuation: ˆ︁∆(1) is not a good interpolation of QCDd for d ∈ C, since it disagrees

with the honest answer as computed directly in d = 3.

Does this mean analytic continuation is not possible? Is there any way to work with

analytic objects ˆ︁∆(1), while at the same time to recover the correct answer ∆(1) when d ∈ N?

In fact, analytic continuation is possible, but the mechanism is not immediately obvious.

To simplify the notation, let us omit the dim(G)/ dim(R) factors (or, equivalently, let us take

G = U(1)). Then, the correct answer in d = 3 is ∆(1) = 256/3π2, as given by (4.1.6) with

tr[γαµν ] tr[γαµν ]/ tr[1]
2 = −3!. On the other hand, the analytic expression (4.1.7) evaluated

at d = 3 reads ˆ︁∆(1) = −128/3π2, which is of course wrong.

The resolution is the following. Close to d = 3, the operator ψ̄ψ becomes degenerate

with ψ̄γµνρψ. This is impossible for generic d, since these operators have different spin, but

in three dimensions one has the low-rank exception γµνρ ∝ ϵµνρ, and therefore these become

the exact same operator. Hence, intuitively speaking, these operators can mix for d close to

3.

If we compute the correction ∆(1) for ψ̄γµνρψ, and force it to be analytic by dropping by
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hand the odd traces tr[γµ1···µn ], we find

ˆ︁∆(1)(ψ̄γµνρψ) =
8(d− 4)Γ(d+ 2)

d2(d− 2)2Γ(d/2)3Γ(1− d/2)
(4.1.8)

If we now take d = 3, we find ˆ︁∆(1)(ψ̄γµνρψ) = 256/3π2, which is the correct answer for

∆(1)(ψ̄ψ). In this way, we recover the correct scaling dimension, as computed honestly in

d = 3, from an object ˆ︁∆(1) that is analytic. But do note that (4.1.8) disagrees with ∆(1)(ψ̄ψ)

at d = 2, so one should not think of this expression as the correct analytic continuation of

∆(1)(ψ̄ψ) for all d ∈ C: this branch is only correct for d close to 3.

This last statement will perhaps be more clear if we plot the analytic dimensionsˆ︁∆(1)(ψ̄γµ1···µnψ) for d ∈ R: where the red dots correspond to the honest value of ∆(1)(ψ̄ψ) as

1.5 2.0 2.5 3.0 3.5 4.0

-5

5

10

d

ˆ︁∆(1)

ψ̄ψ

ψ̄γµ1µ2ψ

ψ̄γµ1µ2µ3ψ

Figure 4.1: The leading 1/Nf corrections ˆ︁∆(1) to the scaling dimensions of ψ̄ψ, ψ̄γµ1µ2ψ, and

ψ̄γµ1µ2µ3ψ as functions of the spacetime dimension d.

computed in integer d, using the rigorous gamma matrix traces in that dimension, without

throwing away odd traces. The solid lines, on the other hand, correspond to ˆ︁∆(1), i.e.,

they are the analytic scaling dimensions that arise after setting tr[γµνρ] ≡ 0 by hand. This

picture makes it clear that all red dots agree with some analytic branch, but no branch is

correct for all dots.

To order 1/ dim(R) the expression for ∆(ψ̄ψ) only includes the trace tr[γµνρ], which is why

this quantity requires only one new branch, around d = 3. To order in 1/ dim(R)2 one finds
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a new trace tr[γµνρστ ] tr[γ
µνρστ ] in the honest, general d expression for ∆(ψ̄ψ). As before, we

can make ∆(2) analytic in d by dropping these odd traces, producing an expression ˆ︁∆(2)(ψ̄ψ)

that agrees with ∆(2)(ψ̄ψ) for all d > 5, but fails otherwise. One can anyway recover the

correct answer at d = 5 by considering the operator ψ̄γµνρστψ, which becomes isomorphic

to ψ̄ψ when d = 5; this gives rise to a new branch, defined around this integer. The “all

orders” exact answer ∆(ψ̄ψ) involves infinitely many branches, one adapted to each odd d,

as a result of the infinitely many exceptional traces tr[γµ1···µn ].

To the extent that a continuation of chiral quantities is well-defined, we expect operators

like ψ̄γ⋆ψ to present discontinuities at the even integers, as a result of the exceptional traces

tr[γ⋆γµ1···µn ]. We do not explore these chiral quantities further here.

In a general CFT, there is no single expression for ∆(O) that is both analytic in d and

that agrees with the correct, honest answer for all d ∈ N. Instead, there is an infinite family

of expressions ˆ︁∆(Oi), where Oi are all the operators that become isomorphic to O at some

d ∈ N. These ˆ︁∆’s are defined by ignoring by hand low-rank exceptions and, as such, they

are all analytic in d. But at the same time, they also capture the correct value of ∆(O)

for those integer dimensions d in which Oi = O. This allows us to have our cake and eat

it too: we can work with analytic objects ˆ︁∆ which, at the same time, contain all the same

information as the honest ∆’s. The only price one has to pay is that one has to choose the

correct branch adapted to each d ∈ N.

Presumably, a similar branched structure exists for all CFT data, and not just scaling

dimensions. We leave a more thorough analysis of this for future work; the confusing five-

point function of ψ̄ψ (cf. (4.1.2)) should be a good place to start.

If the flavor symmetry of the theory has a stable representation theory (e.g., if we consider

parity-even operators in an O(d)-invariant QFT), then there are no low-rank isomorphisms,

and hence no spin degeneracy. In this case, quantities like ∆(O) are single-valued; this is

why “simple theories” like Wilson-Fisher have scaling dimensions that are analytic in d.

The plan for the rest of this paper is as follows. In section 4.2 we make an attempt at

defining the problem more precisely, and we also describe some of the complications that
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arise in a general QFT. In section 4.3 we illustrate these observations by computing a few

observables in a specific theory, viz. QCD. In section 4.4 we study analogous observables in

the QED Gross–Neveu–Yukawa model, including the effects of four-fermion interactions. In

section 4.5 we finish with some open problems and general speculations.

4.2 Generalities

In this section we try to set up the problem of analytic continuation more systematically

and precisely.

4.2.1 Definition (or lack thereof)

Let us begin with the important clarification that we do not claim every QFT admits analytic

continuation, nor that this continuation is necessarily unique. For example, it might be the

case that Chern-Simons theories are stuck to d = 3, but it might also be the case that some

clever re-writing allows us to define them for general d ∈ C. However unlikely the second

one might sound, either option is logically possible, and we make no claim either way.

As for uniqueness, this depends on how one formulates the question. For example, 3d

Maxwell should admit several natural extensions away from d = 3: it is connected to 4d

Maxwell in the obvious way, but also to a 4d compact scalar, since fµν ↔ ϵµνσ∂
σϕ in d = 3.

More generally, analytic continuation of a given QFTd is always relative to a choice of target

at d±1, it is not an intrinsic operation one can perform on a specific QFT. Whenever we talk

about analytic continuation in d, we must choose a sequence of QFTs defined for multiple

integers d ∈ N, and then ask whether they can be interpolated via d ∈ C.

In fact, if uniqueness is to hold at all, it can only do so if we have a target for all d ∈ N,

and not just for a few consecutive integers. Indeed, assume that a certain computation

produces the expression δµνδµν . The obvious analytic continuation is that δµνδµν = d. But

if we only require the continuation to give the right answer for d = 2 and d = 3, then we can

write δµνδµν = f(d) where f(d) is any analytic function that satisfies f(2) = 2, f(3) = 3.
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There are infinitely many such functions, and therefore this construction is not unique. Only

if we impose f(d) = d for all d ∈ N (together with some further constraints on the growth

of f in the complex plane) is the equality f(d) = d for all d ∈ C unique.4 This is of course

a simplified version of the well-known theorem [287] that the usual rules of dim-reg lead to

a unique analytic continuation only if we require them to be correct for all d ∈ N.

An analogous statement holds for continuation of flavor symmetries: we need to specify an

infinite sequence of O(N)-symmetric QFTs to analytically continue N . Any finite collection

of QFTs can always be made part of infinitely many sequences, and they can all be used

to define continuations. As will hopefully become clear as we go on, analytic continuation

in N and in d are not entirely independent operations, and there are many conceptual

similarities. As a very simple example, note that upon compactification (on a sufficiently

symmetric manifold), the Lorentz group becomes a flavor symmetry.

With this in mind, a very rough, intuitive definition could look something like this. Given

an infinite sequence of QFTs defined for all d ∈ N, one computes a certain observable, such

as a scaling dimension ∆d, for all d ∈ N. Then, if this sequence is sufficiently well-behaved

in some sense (such as having bounded forward differences), then it has a unique analytic

continuation to complex d, and we declare that this is the observable the QFT computes at

fractional d.

Of course this is too vague to be an actual definition. For starters, a QFT is not just a

collection of numbers {∆}, but a much richer structure that implies infinitely many coherence

relations between them. Unfortunately, the honest answer is that we don’t have a general

definition. We can mention a few special cases here where a working definition exists, but

we will spend the rest of this paper explaining some of the obstructions associated to this

operation and why the problem is still very much open.

4The precise statement is the following. Say we have a quantity f(d) defined for multiple integers S ⊊ N,
and we wish to continue it to some analytic function on some open, connected set D ⊂ C that contains these
integers. Is this continuation unique? The answer is clearly no: we can always shift f(d) by, say, sin(πd).
The only situation where we can guarantee uniqueness is when S has an accumulation point in D. And the
only accumulation point in N (as embedded in the Riemann sphere C∪ {∞}) is d = ∞. Therefore, the only
way to ensure that f(d) has a unique continuation is to assume that it is defined for all sufficiently large
d ∈ N.
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One situation where rigorous analytic continuation to fractional d may be possible is for

QFTs that admit a lattice discretization [288–298]. These can put on a lattice whose contin-

uum limit has fractional Hausdorff dimension, and this gives a non-perturbative definition

of the field theory at that d ∈ R. A natural question is whether this continuum limit always

exists, whether it is unique, and whether the result is actually analytic in d. We do not

know the answer to any of these questions. Another important issue is how to define this

continuation in theories that do not admit a nice discretization; as we shall see, fermions are

particularly subtle in fractional dimension, precisely for the same reason these objects refuse

to sit peacefully on a lattice.

As for analytic continuation directly in the continuum, we only know how to define

this in perturbative settings. For example, the O(N) model admits a 1/N expansion, and

this perturbative series happens to be analytic in d. Indeed, the large N expansion is

organized in terms of Feynman integrals, and these admit a general definition of analytic

continuation [287].

So, to summarize:

• We do not have a general definition of analytic continuation in d, nor in N . There are

some cases where one can give a working prescription, but these are very non-generic

and it is not clear if the result is always well-defined and unique.

• If a general definition exists at all, it will only lead to a unique extension if we choose

an infinite sequence of QFTs as our starting point. This holds both for analytic con-

tinuation of d and N .

• Not every infinite sequence admits a continuation. Indeed, there is no reason to expect

a random sequence like T (1) = Ising, T (2) = SU(2) + ψadj, T (3) = abelian Higgs,

etc. to admit a meaningful interpolation.
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4.2.2 Kinematics

As above, there is no general definition of analytic continuation of a QFT to d ∈ C. We can

try to make some progress by disentangling the dynamics from the kinematics. Namely, here

we would like to understand the representation theory of the Lorentz group at fractional d.

We begin with the Lorentz group being O(d), and then explain why other global forms such

as SO(d) and Spin(d) do not really have a satisfactory continuation.

Orthogonal group O(d). We first recall some basic facts about Rep(O(d)) [299]. When d

is odd, any irreducible representation can be specified by an SO(d) irreducible representation

λ ∈ Rep(SO(d)), together with a choice of intrinsic parity ±. When d is even, SO(d) has

a Z2 outer automorphism C that permutes the last two Dynkin labels. Then, if λ is fixed

by this action, it induces two representations of O(d) which take the same form as before,

(λ,±). If λ ∈ Rep(SO(d)) is not fixed by C, only the direct sum λ + λC induces an O(d)

representation. We call (λ,+) a true tensor and (λ,−) a pseudo-tensor. For representations

of type λ + λC, there is no intrinsic parity (the two choices for this sign are exchanged by

electric-magnetic duality).

We now explain what the analogue of Rep(O(d)) in the case of fractional d is. The

precise mathematical framework to understand groups of continuous rank is that of Deligne

categories [300]; see [238] for a physics-oriented presentation. Here we simply summarize

some facts about Deligne categories without providing precise definitions; see the references

for more details.

In short, an irreducible representation of O(d) at fractional d is a simple object in the

category ˜︃Rep(O(d)). Such objects are labeled by terminating sequences of non-negative

integers, which play the role of the usual Dynkin labels for integer d.

For convenience we will denote these sequences via the associated Young diagram. For

example, the vector of ˜︃Rep(O(d)) corresponds to the sequence [1] = (1, 0, . . . ). It becomes

a true vector of O(d) when d ∈ N; we will explain how to recover pseudo-tensors below.
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The dimension of a given object in ˜︃Rep(O(d)) can be obtained by plugging its Dynkin la-

bels into the regular Weyl formula of O(d) for increasing values of d ∈ N; this produces

an integer sequence of polynomial growth which, by standard arguments, has a unique

analytic continuation to d ∈ C. For example, the vector representation of O(d) has di-

mension 1, 2, 3, . . . for d = 1, 2, 3, . . . , and this has a unique analytic continuation to the

Riemann sphere, namely f(d) = d. Then, the dimension of the object labeled by (1, 0, . . . )

is dim([1]) = d for all d ∈ C.

Conversely, any sequence of true-tensor representations of O(d) that share the same

Young diagram for all d ∈ N defines an object in the Deligne category above. We will call

such sequences stable. An example of an unstable sequence is Sd[1]: this has d boxes, which

increases as we increase d. The dimension of this sequence is dim(Sd[1]) =
(︁
2d−1
d

)︁
−
(︁
2d−3
d−2

)︁
,

which grows like ∼ 22d, too fast to have a good, unique continuation to d ∈ C. The category˜︃Rep(O(d)) only describes stable sequences, precisely because these, and only these, have a

unique analytic continuation to complex d.

Let us stress that the Deligne category above is not the “Rep” of anything: there is

no structure O(d), d ∈ C, whose category of representations coincides with ˜︃Rep(O(d)). In

order to talk about O(d) at fractional d we do not literally consider a Lie group of complex

rank; instead, it is enough to understand O(d) for all d ∈ N. (Intuitively, ˜︃Rep(O(d)) is a

regularized version of the representation category of the direct limit O(∞).)

The objects in ˜︃Rep(O(d)) can be composed, which generalizes the usual notion of ten-

sor product of representations. In practice, composition looks exactly like regular tensor

products as computed in any O(d) for d ∈ N large enough to fit the representations. For

example,

[1,1]× [1,1] = 1+ [1,1]+ [2]+ [2,2]+ [2,1,1]+ [1,1,1,1] (4.2.1)

holds for all integers d ≥ 11, and therefore it is also true in ˜︃Rep(O(d)).
The category ˜︃Rep(O(d)) allows us to meaningfully talk about tensor fields at fractional d.

An important question is how it relates to Rep(O(d)) when d happens to be an integer. These

are not identical on the nose since, for example, ∧4[1] is a non-trivial object in ˜︃Rep(O(d)) for
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any d, but it is the zero object in Rep(O(3)). The short answer is that, if d ∈ N, there is an

equivalence of categories Rep(O(d)) ∼= ˜︃Rep(O(d))/I where I is the collection of “negligible

morphisms” — the quotient kills all objects in ˜︃Rep(O(d)) that are trivial in Rep(O(d)).

A followup question is what happens to the pseudo-tensors of O(d), which are not

naturally described by ˜︃Rep(O(d)). The answer is that they “reappear” when we quotient

by the null representations above. To see this, note that any pseudo-tensor can equiva-

lently be written as the product of a true tensor and the Levi-Civita symbol. For example

([2],−) ∼= ([2,1],+) when d = 3, ([2],−) ∼= ([2,1,1],+) when d = 4, etc. Therefore, for

any fixed d ∈ N, the pseudo-tensor ([2],−) is described by a certain object in ˜︃Rep(O(d)):
[2,1] when d = 3, [2,1,1] when d = 4, etc.

In this sense, the Deligne category is not “missing” any O(d) representation: for any fixed

d ∈ N, there is some object in ˜︃Rep(O(d)) that descends to any given pseudo-tensor. But

at the same time there is no meaningful way to talk about pseudo-tensors for d ∈ C \ N.

As far as this categorical framework is concerned, only true tensors make sense for general

d ∈ C; pseudo-tensors only reappear when d ∈ N. (An analogous statement holds for

representations of type λ+λC. These do not correspond to any object in ˜︃Rep(O(d)) but, for

any given d ∈ N, there is some object that descends to λ+λC. An example of a tensor of this

type is the (d/2)-form. This does not correspond to an object in ˜︃Rep(O(d)) since its Dynkin

labels are (0, . . . , 0, 2, 0)⊕ (0, . . . , 0, 0, 2), which does not have a meaningful direct limit, this

is not a terminating sequence. But this (d/2)-form does have an image when d ∈ N: ∧2[1]

when d = 4, ∧3[1] when d = 6, etc.)

In conclusion, the category ˜︃Rep(O(d)) captures all representations of O(d) and, for stable,

true tensors, it gives their canonical continuation to d ∈ C. We can anticipate that, in QFT,

pseudo-tensors and tensors whose spin depends on d (say, some field that transforms as

Sd[1]) will both fight back if we try to continue them to fractional d. Only fields that are

true tensors and that define stable sequences as we vary d ∈ N should have a nice analytic

continuation. So for example, the generalization of free Maxwell where the gauge field is

a p-form should be amenable to analytic continuation for any fixed p, but if we want a
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generalization of the theta term, we should take p = d/2, in which case the theory will likely

protest.

Other groups: SO(d), Spin(d), etc. Let us now discuss what goes wrong if we try to

repeat this story for other global forms of the Lorentz group. For example, say that we try to

define a putative ˜︃Rep(SO(d)) via stable sequences of SO(d) representations, i.e., we assume

that its simple objects are again labeled by terminating sequences of non-negative integers.

One problem with this is that, unlike ˜︃Rep(O(d)), our naive ˜︃Rep(SO(d)) is actually missing

some representations. In the case of O(d) we explained that there is no simple object in˜︃Rep(O(d)) that corresponds to the (d/2)-form but, for any fixed d ∈ N, this representation

does have an image: ∧2[1] when d = 4, ∧3[1] when d = 6, etc. On the other hand, in the

case of SO(d), this (d/2)-form is actually reducible, and we can break it into the self-dual

and anti-self-dual parts. These irreducible pieces do not have an image in our ˜︃Rep(SO(d))
at all. (And indeed, it was already noticed in the early days of dim-reg that (anti-)self-dual

fields are especially tricky to analytically continue [301].)

Another problem with this naive definition is that certain operations, like tensor products,

are non-analytic in d. For example, consider the decomposition (4.2.1). This equation is true

in SO(d) for all d ≥ 11, and therefore we would guess that it is also true in ˜︃Rep(SO(d))
for all d ∈ C. But then, we would conclude that [1,1]× [1,1] contains only one singlet for

any d ∈ C, which is actually false: in SO(4) one has ∧4[1] ∼= 1, and therefore there are two

singlets when d = 4. In a formal sense, objects like Hom(R1, R2) in the would-be category˜︃Rep(SO(d)) are discontinuous in d, due to low-rank exceptions.

In fact, the same non-analyticity would occur in ˜︃Rep(O(d)) if we insisted that this cat-

egory should describe pseudo-tensors as well. Indeed, one has ([1,1],−) × ([1,1],+) =

(1,−)+ (∧4[1],−)+ · · · in O(d) for all d ≥ 11, which would imply that there are no singlets

for any d ∈ C, which is actually false: when d = 4, there is one singlet, since in this case

(∧4[1],−) ∼= (1,+). True tensors are stable, pseudo-tensors are not.

Finally, let us consider the Spin(d) form of the Lorentz group. This group has the same
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issues as SO(d): self-dual and anti-self-dual representations are not captured by terminating

sequences of Dynkin labels at all, and low-rank exceptions make tensor products non-analytic

in d. One could wonder if Pin(d) might fare better, since O(d) does admit a continuation as

opposed to SO(d). The answer is no, not really : pinor representations are also not captured

by terminating sequences of Dynkin labels. Indeed, this representation has Dynkin labels

(0, . . . , 0, 1) for odd d, and (0, . . . , 0, 1, 0)⊕ (0, . . . , 0, 0, 1) for even d, and these sequences do

not have a meaningful direct limit. Pinors are unstable representations. For example, their

dimension 2⌊d/2⌋ is non-polynomial in d and, as such, it does not have a well-defined, unique

continuation to d ∈ C5.

As a well-known example of the complications associated to pinors, consider the trace

tr[γµνρ]. If we compute this for small values of d, we find

d = 2: tr[γµνρ] = 0

d = 3: tr[γµνρ] = 2iϵµνρ

d = 4: tr[γµνρ] = 0

d = 5: tr[γµνρ] = 0

...

(4.2.2)

whose stable limit is tr[γµνρ] = 0. This is the standard ’t Hooft-Veltman prescription for this

trace; while correct around d = 4, it gives the wrong answer for the small rank exception

d = 3. This means that if we use this continuation for d ∈ C, we will necessarily get

the wrong answer when we take d → 3. More generally, all prescriptions for fermions in

fractional dimension found in the literature ignore by hand low-rank exceptions that occur

below d = 4, which means that they will necessarily fail for small enough d. If our only goal

is to continue to an infinitesimal neighborhood of d = 4, this is not the end of the world, but

5A possible formalization of these facts, suggested to us by Justin Kulp, is the following. As above,˜︃Rep(O(d)) is the correct category to talk about stable representations. On the other hand, unstable repre-
sentations are not objects in this category. But, the fact that unstable representations can be tensored to
produce stable ones (e.g., the square of a pinor is 1 + [1] + ∧2[1] + · · · ) means that these large represen-
tations should be objects in a module category of ˜︃Rep(O(d)), i.e., what we are missing is some version of˜︃Rep(Cliff(d)) as a module over ˜︃Rep(O(d)). See also [302] (and in particular the discussion around footnote
8).
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if we want a continuation to d ∈ C that gives the correct answer when d = 3 or d = 2, we

cannot drop small d exceptions, and we have to work harder.

Back to physics. We should note here that the fact that the representation theory of

O(d) is well-defined for non-integer d does not imply that analytic continuation of O(d)-

symmetric QFTs is necessarily easy. For example, scalar fields transform according to the

trivial representation of O(d), which is stable. But, out of these scalars, one can construct

more complicated tensors, including unstable ones. Indeed, consider the evanescent operators

of [240], given by Rp := tr∧p[1][M ], where Mµν = ∂µ∂νϕ. The representations ∧p[1] are all

well-defined for d ∈ C. But if we take d to be an integer, then the operators with p > d are

all null. As such, their continuation to fractional d is rather subtle: for example, they often

have negative norm [240].

For QFTs that are invariant under SO(d) only, things are even less straightforward. The

lack of a proper ˜︃Rep(SO(d)) category means that parity-breaking QFTs cannot be continued

to complex d, at least not if we want to use the framework of Deligne categories as above.

Of course, in physics we never let the lack of a rigorous framework stop us. We should try

to continue such theories anyway; if the results are consistent, then a suitable generalization

of Deligne categories must exist.

In this paper we will only study vector-like theories, but with a focus on parity-odd

operators. Such representations are unstable from the point of view of ˜︃Rep(O(d)), and

therefore they should present the same obstructions as generic operators in a chiral theory.

For example, much like HomSO(d)([1,1] × [1,1],1) = δd,4C is non-analytic in d due to the

SO(4) low-rank isomorphism ∧4[1] ∼= 1, one also has HomO(d)(([1,1],+)× ([1,1],−),1) =

δd,4C due to the O(4) low-rank isomorphism (∧4[1],−) ∼= (1,+). These low-rank exceptions

will force us to go beyond the current framework of analytic continuation in QFT.

For completeness, let us mention that this whole discussion also goes through for analytic

continuation of flavor (or gauge) symmetry groups. For example, an O(N) symmetry should

allow for a somewhat straightforward continuation of N , but an SO(N) symmetry will likely
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be harder to define. For a general symmetry group, its Deligne interpolating category is well

defined if its representation theory is stable; the best understood examples [238] are U(N),

Sp(N) and SN . For example, the fact that ˜︃Rep(U(N)) exists but ˜︃Rep(SU(N)) does not is

related to the well-known fact that mesons in planar QCD are much easier to understand

than baryons [303]. The latter are unstable in the sense above: while [1] ⊗ [1] contains

a singlet for any number of colors, there is no finite power of [1] that yields a singlet in

“˜︃Rep(SU(N))”. Unstable representations are non-perturbative in 1/N , and they obstruct

any naive attempts at analytic continuation of this parameter. (Similarly, the existence

of ˜︃Rep(SN) is related to the success of operations like the replica trick and the symmetric

product orbifold).

4.2.3 A simple example: free fermions

As we reviewed above, fields transforming in unstable representations of the Lorentz group

are particularly adverse to analytic continuation, (s)pinors being the most important ex-

ample. Does this mean fermionic theories cannot be analytically continued to d ∈ C? We

believe a meaningful continuation is possible, although we will explain here some of the

obstructions one has to overcome, and then describe our best attempts at doing so.

Here we will frame the discussion in the context of free Dirac fermions. We will perform

a few computations in this QFT and then ask whether the result admits a meaningful con-

tinuation or not. This is an extended version of the toy model discussed in the introduction;

readers interested in the interacting case only can safely skip to section 4.3.

A simple observable one can consider is the free energy of this system. This quantity is

given by [304]

logZ = 2⌊d/2⌋+2−d
∞∑︂
n=1

(−1)n+1

n
sinh(n/2T )1−d (4.2.3)

Does this admit a meaningful continuation to complex d? The factor 2⌊d/2⌋ doesn’t seem to

like d ̸∈ N, but this is obviously a moot point: we could just as well ask about the free energy

per fermionic degree of freedom, which simply amounts to dividing the expression above by
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this awkward factor. The resulting object does admit a perfectly healthy continuation to

complex d. (And note that one can extract some interesting physics already for this extremely

simple observable: for example, the limits T → 0 and d → 1 do not commute. This reflects

the fact that the ground state is discontinuous at d = 1: there is only one vacuum for d > 1,

but two vacua at d = 1.)

Are there observables for which analytic continuation is not possible? A potential example

is the following. Give the fermion a mass m, and couple it to a background U(1) gauge field

A. At energies below m we can integrate out the fermion, producing a local effective action

for A [305, 306]:

Seff(A) ⊃ Tr log(/∂ +m+ i /A)

= Tr log(/∂ +m) + Tr

[︃
1

/∂ +m
i /A

]︃
− 1

2
Tr

[︃
1

/∂ +m
i /A

1

/∂ +m
i /A

]︃
+ · · ·

(4.2.4)

The parity-even part of this effective action is straightforward. For example, at the

quadratic level O(A2), it reads6

Seven
eff (A) ⊃ 1

2

∫︂
k

Aµ(k)Aν(−k)
∫︂
p

tr[S(p)γµS(p+ k)γν ]even (4.2.5)

where

tr[S(p)γµS(p+ k)γν ]even =
−1

(p2 +m2)((p+ k)2 +m2)

(︁
tr[/pγ

µ(/p+ /k)γν ]−m2 tr[γµγν ]
)︁

tr[S(p)γµS(p+ k)γν ]odd =
−im

(p2 +m2)((p+ k)2 +m2)

(︁
tr[/pγ

µγν ] + tr[γµ(/p+ /k)γν ]
)︁
(4.2.6)

Evaluating the trace and performing the p integral7, we learn that the heavy fermion simply

generates a renormalization of the would-be gauge coupling:

Seven
eff (A) ⊃ 2⌊d/2⌋

Γ(2− d/2)

3(4π)d/2
|m|d−4

∫︂
k

1

2
Aµ(k)(k

µkν − k2δµν)Aν(−k) (4.2.7)

6We denote momentum integrals by
∫︁
k
:=
∫︁

ddk
(2π)d

and the free fermion propagator by S(p) = 1
i/p+m .

7Here we neglect the question of whether such momentum integrals converge in the first place. While
very important in general, and even more so in the context of varying d, this issue is orthogonal to the one
we are trying to address here. So below we just cut off the integrals at p = Λ and consider m≫ Λ ≫ k, and
throw away subleading terms like Λ/m.

119



Up to the inconsequential factor 2⌊d/2⌋, this admits a natural analytic continuation to d ∈ C.

The parity-odd part in Seff(A) is a very different story. For example, at the linear level

O(A) we find

Sodd
eff (A) ⊃ i

∫︂
k

Aµ(k)

∫︂
p

tr[S(p)γµ]

= i tr[γµ] sign(m)|m|d−1Γ(1− d/2)

(4π)d/2

∫︂
k

Aµ(k)

(4.2.8)

Now, while the coefficient Γ(1−d/2)
(4π)d/2

admits a meaningful continuation to d ∈ C, things

are not so simple for the trace tr[γµ]. In d = 1 this is just tr[γµ] = ±1, and we obtain

the well-known 1d Chern-Simons term that arises when integrating out a heavy fermion:

Sodd
eff (A) ⊃ i

2
sign(m)

∫︁
A. If d is an integer different from 1, this trace vanishes instead. So,

for general d ∈ N, the effective action contains a Kronecker delta δd,1, and there is no natural

way to analytically continue such an object to fractional d. Similarly, at the quadratic level

we find something proportional to tr[γµνρ] ∝ δd,3ϵ
µνρ, for which there is no obvious analytic

continuation either. And of course the pattern continues: there is a 5d Chern-Simons term

at the cubic level, etc.

So even for this very simple theory, which is free and vector-like, it is not entirely clear

how to continue away from integer dimensions. Some questions, like the free energy, are

well-defined for d ∈ C; some others, like the free energy in presence of an external field,

not quite so. And we see that the main obstruction is the existence of low-rank exceptions.

Indeed, the even part of Seff(A) only involves traces of an even number of gammas, and these

are the same for all d; but the odd part involves traces with an odd number of gammas, and

those vanish unless the number of insertions equals the number of spacetime dimensions. In

other words, Seven
eff (A) has a stable limit (and it agrees with it) but Sodd

eff (A) does not.

One could complain that the issue with this analysis is that we are trying to analytically

continue an object, Seff(A), which is a function of a vector field, and it is sort of meaningless

to talk about non-trivial tensors in fractional dimension anyway; only scalars are to be

continued. This is not entirely true since, as we explained above, stable tensor fields make

sense in fractional dimension, and vectors are stable. But in any case, there are complications

120



for scalar questions as well, as we explain next.

For simplicity let us turn off A and let us set the fermion mass to zero, and consider

the correlation functions of ψ̄ψ. This operator is parity-odd8, so we might expect the same

difficulties as above; but crucially, it is a Lorentz scalar, so if we find any obstacles to

analytically continuing its correlators, those will be harder to dismiss. We can begin with

its expectation value, which is given by

= − lim
x→0

tr[S(x)]

=
Γ(d/2)

2πd/2
tr[γµ] lim

x→0

xµ

xd

(4.2.9)

which contains once again the problematic tr[γµ] factor. This trace vanishes for all integers

d > 1. But in d = 1 the trace is non-zero and we find ⟨ψ̄ψ⟩ = 1
2
δ1,d. Again, it is unclear how

this should be analytically continued in d.

There is a simple explanation for this discontinuity at d = 1. This operator has scaling

dimension ∆(ψ̄ψ) = d − 1. For d > 1, this is non-zero, and its vev is forced to vanish by

the (unbroken) scaling symmetry. But in d = 1 the scaling dimension vanishes, and this

operator becomes degenerate with the identity, which allows for mixing of these operators,

explaining why ψ̄ψ is allowed to acquire a vev. This mixing is a discontinuous process and

we should not be alarmed by it. In d = 1 we could define a different operator by subtracting

the contribution of the identity, namely by normal ordering :ψ̄ψ: = ψ̄ψ−1/2, which now has

vanishing vev. Apparently, the reasonable analytic continuation of this expectation value is

⟨ψ̄ψ⟩ = 0 for all d, including d = 1. This is a bit misleading: the combination ψ̄ψ − 1/2

doesn’t make sense above d = 1, since ψ̄ψ has non-zero ∆ (more precisely, this combination

is not a conformal primary). So we either work with ψ̄ψ, which has a discontinuous vev,

or with the discontinuous object ψ̄ψ − δ1,d/2, which has continuous vev. Either way, this

bilinear operator is simply non-analytic in d around d = 1.

8Parity here refers to reflections, namely flipping the sign of a single spatial coordinate, say, x1. This
acts as ψ ↦→ γ1ψ and ψ̄ ↦→ −ψ̄γ1 (the relative sign is inherited from the Lorentzian identification ψ̄ = ψ†γ0).
The usual mass term ψ̄ψ is odd under reflections. In even dimensions, one can also consider ψ̄γ⋆ψ, which is
even.
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Are there any further discontinuities in ψ̄ψ at higher d? We can answer this question by

looking at its connected five-point function

x1

x5
x4

x3
x2

+ permutations (4.2.10)

for a total of 4! = 24 permutations. The first permutation is proportional to(︃ 5∏︂
i=1

(xi − xi+1)µi
|xi − xi+1|d

)︃
tr[γµ1γµ2γµ3γµ4γµ5 ] (4.2.11)

We can use the Clifford relation to write the product of five gammas as the fully anti-

symmetrized product γµ1µ2µ3µ4µ5 , plus terms with three gammas, γµ1µ2µ3δµ4µ5 (plus per-

mutations), and terms with a single gamma, γµ1δµ2µ3δµ4µ5 (plus permutations). The fully

anti-symmetric term γµ1µ2µ3µ4µ5 vanishes due to translation invariance, since we only have

four linearly independent vectors to contract it with. So the final answer is that the five-point

function is proportional to various combinations of the xi’s contracted with tr[γµνρ] ∝ δ3,d

and with tr[γµ] ∝ δ1,d. Although not obvious from this discussion, the overall coefficient is

non-zero, i.e., the various combinations do not cancel each other out9.

The conclusion of this little exercise is that this correlation function vanishes for all d ∈ N

except for d = 3. Then, the stable limit of this correlation function is that it vanishes for

all d ∈ C, and we again discover a non-analytic behavior of ψ̄ψ, this time not only at d = 1,

but also at d = 3. It is not hard to imagine that the seven-point function is proportional to

the trace of five gammas, giving rise to a discontinuity at d = 5, etc. Not only is the vev of

ψ̄ψ discontinuous as a function of d, so are its higher correlation functions.

For future reference we mention that, if we were interested in quartic operators such

as (ψ̄ψ)2, then there are well-known subtleties such as the existence of operators of the

9The full expression is too large to include here. If we take the simplifying configuration x1 = (0, 0, 0),
x2 = (0, 0, a), x3 = (0, 0, 1), x4 = (0, b, 0), x5 = (c, 0, 0), and take the the limit a → 0, b → ∞ so that the
result fits in a single line, we find

b5|a|⟨ψ̄ψ(x1) · · · ψ̄ψ(x5)⟩ = i sign(c)

(︃
1

c2
− |c|

(1 + c2)3/2

)︃
(4.2.12)

up to factors of 2π. This is of course odd under parity, as required, but crucially non-zero.
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form [307, 308]

On := ψ̄γµ1···µnψ ψ̄γµ1···µnψ (4.2.13)

These are scalars and degenerate with (ψ̄ψ)2, so these operator will generically mix. In

integer dimensions, the operators with n > d vanish by anti-symmetry. But in fractional

dimension these are independent and non-trivial, and one must consider them together with

the original quartic [284, 309, 310]. The quartics with n > d are evanescent: non-trivial

when d ̸∈ N, but null when d ∈ N. The difficulty in defining traces of gamma matrices in

non-integer dimension also shows up in On; for example, the OPE of ψ̄ψ with the quartics

above is

ψ̄ψ(x)On(0) ∼
1

x2(d−1)
tr[γµ1···µn ]ψ̄γ

µ1···µnψ + · · · (4.2.14)

Without a prescription for tr[γµ1···µn ] in fractional dimension, we are somewhat forced to

admit that OPEs are discontinuous as a function of d, even for scalar operators as we are

considering here.

Clearly, even free theories present some difficulties in defining a meaningful continuation

in d. In the reminder of this paper we will study interacting theories instead. But before

doing that, this might be a good point to pause and discuss our conventions for gamma

matrices in fractional dimension.

4.2.3.1 Gamma matrices

Integer dimension. For integer d we define the Clifford algebra as

γµγν + γνγµ = 2δµν (4.2.15)

It is a well-known fact that, if d is an integer and δµν denotes the standard metric on Rd,

then the Clifford algebra admits an (essentially unique) irreducible matrix representation,

of dimension 2⌊d/2⌋ (see e.g. [311]). For the discussion below we don’t need to assume that

the matrix representation has been chosen to be irreducible. In fact, when a QFT contains

Nf fermions, one might as well declare that the theory has a single fermion that transforms

123



under the reducible representation that consists of Nf copies of the irreducible one. This

latter perspective is notationally more convenient, especially in the case of fractional d.

The Clifford relation (4.2.15) implies the usual reduction identities, such as

γµγµ = d

γµγνγµ = (2− d)γν
(4.2.16)

etc. Similarly, one can also take the matrix trace of the Clifford relation, which yields the

usual trace identities

tr[γµγν ] = δµν tr[1]

tr[γµγνγργσ] = (δµνδρσ − δµρδνσ + δµσδνρ) tr[1]
(4.2.17)

etc.

Traces over the odd part of Clifford are a little less well-behaved. First, we can use the

Clifford relation to write a product of gamma matrices as their full anti-symmetrization, plus

products of fewer matrices. For example,

γµγνγρ = γµνρ + γµδνρ − γνδµρ + γρδµν (4.2.18)

where γµνρ := 1
3!
(γµγνγρ±permutations). Therefore, we only need to work out traces of fully

anti-symmetrized gammas tr[γµ1···µn ] since more general products can always be reduced to

these.

As is well-known, tr[γµ1···µn ] vanishes unless n is equal to d and is also odd. This follows

from the basic identity

γαγ
µ1···µnγα = (−1)n(d− 2n)γµ1···µn (4.2.19)

together with cyclicity. When this trace is non-zero, it equals ±i(n−1)/2ϵµ1···µn tr[1]. The sign

is arbitrary, since ±γµ both satisfy the Clifford algebra. This sign can be understood as

a choice of orientation; it does not affect the even part of the algebra, which is why both

choices lead to the same representation of Spin(d).
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Fractional d. As explained in subsection 4.2.2, fractional d does not literally mean that

the rank of O(d) is fractional. Instead, we are instructed to look at the Deligne category˜︃Rep(O(d)). Unfortunately, the fermionic version ˜︃Rep(Pin(d)) is not actually well-defined:

pinor representations are unstable.

We of course do not want to admit defeat either, so let us push through anyway. In-

tuitively, fractional d should look something like Rep(Pin(∞)). We will not try to make

this precise, but we do ask: is there any sense in which the various formulas like (4.2.16)

and (4.2.17) have a direct limit? If not in the rigorous mathematical sense, at least in a more

practical one?

In fact, some formulas do admit a meaningful stabilization. For example, the relation

γµγνγµ = (2− d)γν is true for all d ∈ N, and therefore it makes sense to claim that it is also

true when d ∈ C. In order to make this rigorous one would have to specify what type of

object γµ is when d ∈ C. We will not let these minutiae distract us too much; in practice, one

can regard these matrices as elements of a formal algebra of symbols subject to the Clifford

relation.

What about the identity tr[γµγν ] = δµν tr[1]? This equation is again true for all d ∈ N,

so it is tempting to once again declare that it is also true when d ∈ C. This is not entirely

immediate though:

• If we think of the γµ’s as living in a certain algebra of symbols, then this trace

identity formally follows from the Clifford relation, as long as “tr” satisfies linearity

tr[λA+µB] = λ tr[A] +µ tr[B] and cyclicity tr[AB] = tr[BA]. But this is not actually

well-defined, since there is no sense in which such an algebra has a finite-dimensional

representation, and therefore there is no reason a trace acting on it should exist.

• Relatedly, the trace relation looks stable when written in terms of tr[1]. But if we

replace this factor by 2⌊d/2⌋, the identity no longer looks particularly nice, since this

sequence does not have a unique analytic continuation.

One can formally fix both problems at the same time by writing instead tr[γµγν ]/ tr[1] =
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δµν . Now, the l.h.s. can be thought of as a “regularized trace”, one that has a finite d → ∞

limit, and the r.h.s. is a perfectly well-defined, stable tensor. In practice, this just means

that the trace relations over the even part of the Clifford algebra are all correct at fractional

d, but with the understanding that the factor tr[1] is to be left as is, instead of replacing it

by 2⌊d/2⌋ or some interpolation thereof.

This last comment actually has an important corollary. When we work with Dirac

fermions in a certain integer-dimensional QFT, we take ψ to transform according to a pinor

representation of the Lorentz group. Such a representation is always given by a certain

number of copies of the irreducible, 2⌊d/2⌋-dimensional representation, and we define Nf to

be this number. In other words, “number of fermions” in a given QFT simply means how

many copies of the smallest Dirac representation appear in our theory. In fractional d, there

is no such “smallest” representation, and therefore no canonical definition of Nf . The object

that plays the role of Nf is tr[1], where the trace refers to a sum over both flavor and spin

indices. If one wishes to specialize our general-d formulas to a given d ∈ N, the dictionary is

tr[1] = Nf × 2⌊d/2⌋ (4.2.20)

If d ̸∈ N, there is no canonical way to disentangle spin and flavor, and the only meaningful

operation is tracing over both, at the same time. Therefore, in the same way Nf normally

labels families of fermionic QFTs, in fractional dimension it is tr[1] what labels such families.

The traces over the odd part of Clifford are again less well-behaved. Indeed, the identity

tr[γµ1···µn ] = ±δn,di(n−1)/2ϵµ1···µn tr[1] implies that (for fixed n) these traces all vanish for

sufficiently large d, and therefore their stable limit is that they vanish for all d ∈ C. But of

course setting them to zero does not lead to a good analytic continuation, since they miss

the low-rank exceptions where these traces are occasionally non-zero.

For the time being, we will simply leave the odd traces unspecified. That is to say, in

the same way the factor tr[1] is not meant to be continued to d ∈ C, but just carried along,

the odd traces tr[γµ1···µn ] will also be left as is. As we shall see, one can get very far without

ever trying to write down a specific formula for these traces.
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The rules above are enough to have a working theory of fermions in fractional dimension.

Our general philosophy is that, if one wants to be on the safe side when working with gamma

matrices, the parameter d is always an integer, there is no such a thing as γµ ∈ Pin(d) for

d ∈ C. Instead, one computes observables using formulas that are true for all d ∈ N, and

analytically continues the answer, not the intermediate steps. (It goes without saying, this

last part is still very non-trivial, and not even necessarily well-defined; here we are just

kicking the can down the road.)

Conversely, if one insists on trying to work with formal symbols defined for all d ∈ C, one

runs into many well-known paradoxes. Let us describe a few of them here for illustration

purposes. In the discussion below we abandon our general philosophy that one should only

talk about γµ for integer d, and assume that these exist at fractional d as well.

If γµ is a valid object at fractional d, and “tr” is a valid operation acting on it, then we

must admit the existence of a symbol tr[γµ]. This is non-zero for d = 1, and therefore we

cannot just claim that tr[γµ] = 0 for all d ∈ C. For example, it might be the case that

tr[γµ] tr[γµ]
?
=

1

Γ(d)Γ(2− d)
(4.2.21)

or some other analytic function of d that equals δ1,d when d ∈ N.

One can in fact give a formal argument to determine tr[γµ] for fractional d. First, note

that this symbol satisfies the identity

tr[γρ]δµν = tr[γµ]δνρ = tr[γν ]δµρ (4.2.22)

as can be checked by taking the trace of (4.2.18) and using cyclicity. By contracting µ

and ν one finds d tr[γρ] = tr[γρ] which implies that either d = 1 or tr[γρ] = 0. This is of

course the correct answer for integer d, but also appears to follow from the Clifford relation

for fractional d as well. Therefore, if we take the point of view that gamma matrices for

fractional d are well-defined as formal symbols, and that their traces are meaningful as formal

operations that satisfy linearity and cyclicity, then tr[γρ] is identically zero at fractional d.

In other words, the only possible value we can assign to this symbol that is compatible with

the standard properties of “tr” is tr[γµ] tr[γµ] = δ1,d, which is non-analytic in d.
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Of course, another solution to d tr[γρ] = tr[γρ] is tr[γρ] = ∞, which is perhaps the only

logical trace for an object that is not trace class. This also nicely matches the intuition that

fractional d is formally equivalent to infinite d.

The identity (4.2.22), while admittedly rather weird, seems to be required for consistency

of momentum integrals. For example, we typically say that, under the integral sign, kµkµ →
1
d
δµνk2, since δµν is the only tensor that has the right index structure. But if we admit

that tr[γµ] is a valid tensor, one should aslo allow for tr[γµ] tr[γν ], which technically is also

a symmetric rank-2 tensor. The identity (4.2.22) implies that these are not independent

structures: indeed, multiplying both sides by tr[γν ], we find tr[γµ] tr[γν ] = δµν tr[γρ] tr[γ
ρ].

So at the very least, these formal manipulations do not interfere with the standard rules of

analytic continuation of loop integrals.

While the argument above concerns the trace of a single gamma, the same pattern occurs

for any odd number of gammas. For example, once again using Clifford plus cyclicity, one

can check that

δµρ tr[γνστ ] + δνσ tr[γµρτ ] + δµτ tr[γνρσ]− δνρ tr[γµστ ]− δµσ tr[γνρτ ]− δντ tr[γµρσ] = 0 (4.2.23)

Contracting µ and ρ simplifies to (d − 3) tr[γνστ ] = 0, which again implies that this trace

vanishes unless d = 3. The general statement is that the trace of n gamma matrices, where

n is odd, is proportional to δn,d, even if d is fractional.

Moreover, if we insist that these traces make sense at d ∈ C, there are some further

questions one must reckon with. For example, is the operator tr[γµ]ψ̄γ
µψ a Lorentz scalar?

If the symbol tr[γµ] defines a valid expression with a free Lorentz index, we should be able

to contract it with other free Lorentz indices to construct scalars. More generally, one would

guess that ψ̄ψ is infinitely degenerate with operators of the form

tr[γµ1···µn ]ψ̄γ
µ1···µnψ, n odd (4.2.24)

We will term these operators extraneous. They are similar in spirit to the evanescent oper-

ators (4.2.13) we encountered in the previous subsection, and it is tempting to ascribe the

various discontinuities in ψ̄ψ to their existence.
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These extraneous operators appear in the OPE of the evanescent quartics. For example,

consider the quadratic ψ̄ψ, and compute its OPE with a generic quartic ψ̄Γψ ψ̄Γ̄ψ for a pair

of arbitrary matrices Γ, Γ̄. The double contractions give

ψ̄ψ(x) ψ̄Γψψ̄Γ̄ψ(0) ⊃ tr[S(x)2Γ]ψ̄Γ̄ψ + tr[S(x)2Γ̄]ψ̄Γψ + ψ̄Γ̄S(x)2Γψ − ψ̄ΓS(x)2Γ̄ψ

∝ 1

x2(d−1)

(︁
tr[Γ]ψ̄Γ̄ψ + tr[Γ̄]ψ̄Γψ + ψ̄[Γ̄,Γ]ψ

)︁
(4.2.25)

If we now take Γ = γµ1···µn and Γ̄ = γµ1···µn , the OPE becomes

ψ̄ψ(x)On(0) ⊃
1

x2(d−1)
tr[γµ1···µn ]ψ̄γ

µ1···µnψ (4.2.26)

Therefore, if we admit the existence of the evanescent operators On, it seems somewhat

unavoidable to accept the existence of extraneous operators as well.

All of these paradoxes go away if we agree that the gamma matrices are only defined

for integer d, and the analytic continuation is not defined by literally working in Pin(d) for

d ∈ C, but rather we should study Pin(d) for all d ∈ N, and (roughly speaking) take the

direct limit Pin(∞).

In this work we are only concerned with vector-like theories, and we don’t have much to

say about the chirality matrix γ⋆. This matrix is even more subtle than the regular gamma

matrices. For example, while tr[γµνρ] is hard to define for d ∈ C, at least it has a d → ∞

limit: this trace vanishes for all sufficiently large d. This limit misses the d = 3 low-rank

exception, but at least it exists. On the other hand, tr[γ⋆] oscillates between 0 (for even d)

and tr[1] (for odd d), and therefore it does not even have a limit.

It appears to us that, if an analytic continuation of γ⋆ is possible at all, it will hardly be

unique. For example, if we define for integer d

γ⋆ := id(d−1)/2γ1 · · · γd (4.2.27)

where the factor of i is included to make γ⋆ hermitian, then it follows that

(γ⋆)2 = 1

γµγ
⋆γµ = (−1)d+1dγ⋆ (4.2.28)
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etc. The factor (−1)d+1 does not have a unique, canonical continuation to d ∈ C. Assuming

that these equations make sense in fractional d for some choice of analytic continuation,

then upon taking the formal trace one finds (−1)d+1 tr[γ⋆] = tr[γ⋆]. Therefore, if our choice

of analytic continuation for (−1)d+1 is such that it differs from 1 for d ̸∈ N, then we must

once again conclude that tr[γ⋆] vanishes when d ̸∈ N, and this trace is again non-analytic in

d. Of course, similar conclusions hold for traces containing γ⋆ and one or more insertions of

γµ’s.

One can use γ⋆ to construct further evanescent operators, such as ψ̄(1−(−1)(d
2−1)/8γ⋆)ψ.

Perhaps one has to take these into account as well. We will not explore the matrix γ⋆ any

further in this chapter.

4.3 A case study: QCD

Here we will illustrate the general discussion from the previous section in one particularly

interesting example: vector-like massless QCD. Needless to say, this theory is the prototypical

example of a strongly-coupled QFT. In order to recover computational control we will be

working in the large Nf limit, in which the strongly-coupled, low-energy fixed point becomes

tractable as a series expansion in 1/Nf . We have no insights as to what a non-perturbative

definition should look like.

We use the standard large-Nf expansion and compare the result with the known dynamics

of the theory in d = 1, 2, 3, 4.

In order to simplify the notation, let us restrict ourselves to the abelian case for now; we

will point out the modifications required for general gauge group below. The lagrangian of

the theory in Euclidean signature is given by

L =
1

4e2
fµνfµν − ψ̄γµ(∂µ + iaµ)ψ + gauge-fixing (4.3.1)

As far as the large Nf expansion is concerned, this Lagrangian describes a flow between

the free CFT e2 → 0 and the interacting CFT e2 → ∞. The engineering dimension of e2 is
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4− d, and therefore the direction of the flow depends on whether d is larger or smaller than

4. The interesting case is of course d ≤ 4, but in order to talk about analytic continuation

in d we must choose a target QFT for all d ∈ N, and therefore we will also care about this

theory for d > 4. For simplicity we will use language adapted to d < 4, namely we will

call the e2 → 0 fixed point the “high energy” theory and the e2 → ∞ fixed point the “low

energy” one, even though these roles are exchanged for d > 4. The low-energy theory is

non-perturbative in e2 but weakly-coupled in 1/Nf .

The Feynman rules of this theory at the low-energy fixed point are

= −i /
p

p2

µ ν
=

g

pd−2
(δµν + ξpµpν/p2)

(4.3.2)

together with the usual vertex −iγµ. Here, g is the effective coupling

g :=
(4π)d/2

tr[1]

2Γ(d− 2)

Γ(2− d/2)Γ(d/2− 1)2
d− 1

d− 2
(4.3.3)

where tr[1] = 2⌊d/2⌋Nf . Note that, in position space, the photon propagator is∫︂
k

eikx
g

kd−2
(δµν + ξkµkν/k

2)

=
2

(4π)d/2Γ(d/2)

g

x2
((d− 2 + ξ)δµν − 2ξxµxν/x

2)
(4.3.4)

which has the same 1/x2 scaling as its d = 4 counterpart. This implies that ∆(fµν) = 2,

which is below the unitarity bound d− 2 for all d > 4. The d > 4 CFTs are all non-unitary.

We will compute the following observables to leading order in g ∼ 1/Nf :

• The expectation value of W for various closed contours, where W denotes a Wilson

line:

W (γ) = exp

(︃
i

∮︂
γ

a

)︃
(4.3.5)

• The scaling dimension of ψ. By this we mean the exponent in the two-point function

⟨ψ̄(x)Wψ(0)⟩ ∝ x−2∆(ψ) (4.3.6)
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where W is a Wilson line connecting x to 0. This x dependence arises for a straight

Wilson line, since we want the geometry to preserve scale invariance.

• The scaling dimension of ψ̄ψ, namely the exponent in

⟨ψ̄ψ(x)ψ̄ψ(0)⟩ ∝ x−2∆(ψ̄ψ) (4.3.7)

We will then try to analytically continue these observables to d ∈ C.

Another observable that would be particularly instructive to study in the future is the

magnetic current ⋆f . As above, this satisfies ∆(⋆f) = 2, which saturates the unitarity bound,

in agreement with its being conserved. This operator is parity-odd, which means that it is an

unstable representation of O(d), i.e., its continuation to fractional d is much more involved

than f itself. See for example [312] for some very interesting results concerning magnetic

operators in fractional dimension.

4.3.1 Wilson lines

In this section we sketch the computation of the expectation value of Wilson lines along

various closed contours [313]. This is textbook material by now so we will be superficial; the

main point we want to illustrate here is that these expectation values admit a well-defined

analytic continuation in d.

As mentioned above, we begin with the case of abelian gauge group, and generalize to

arbitrary gauge group afterward.

The expectation value is given by the usual cluster expansion

⟨ei
∮︁
a⟩ = e−

1
2

∮︁ ∮︁
⟨aa⟩+ 1

4!

∮︁ ∮︁ ∮︁ ∮︁
⟨aaaa⟩c+··· (4.3.8)

To leading order in 1/Nf we simply keep the first term. So we need to line-integrate the

propagator ∆µν = ⟨aµaν⟩ along the contour of interest:

log⟨W (γ)⟩ = −1

2

∮︂∮︂
γ×γ

dxµ dyν∆µν(x− y) (4.3.9)
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For the actual computations we use two different regulators: analytic regularization 1
x2

→
µ2

(µ2x2)α
(with µ some arbitrary scale) and point-splitting regularization, where we deform one

integration contour via γ → γ + ϵ. We can gain different insights from each of these two

options.

In this discussion we will write the photon propagator as ∆µν =
δµν

x2
, which accounts for

multiple situations:

• If we multiply by e2

4π2 we obtain free Maxwell in 4d. This will be a useful cross-check

for our computations.

• If we multiply by 4g
(4π)d/2Γ(d/2−1)

, we obtain the low-energy fixed point of QEDd to leading

order in 1/Nf .

• If we replace 1
x2

→ µ2

(µ2x2)α
and take α → d/2 − 1 instead of α → 1, we obtain the

high-energy fixed point of QEDd instead of the low-energy one. The associated short-

distance coupling is e2 = µ4−d 4πd/2

Γ(d/2−1)
.

Let us first explain why we are allowed to use ∆µν ∝ δµν

x2
, without the ξ-dependent part,

instead of the more general ∆µν ∝ 1
x2
((d − 2 + ξ)δµν − 2ξxµxν/x

2) (cf. (4.3.4)). A formal

proof of gauge invariance is as follows. To leading order in 1/Nf , we need to integrate

the propagator along a (flat) closed 2-manifold of the form γ × γ, where γ is the support

of W . Then, under the integral sign, we can replace xµxν → 1
2
δµνx

2, which means that

(d− 2+ ξ)δµν − 2ξxµxν/x
2 → (d− 2)δµν , and the answer is ξ-independent. A perhaps better

argument is to note that, in momentum space∮︂
γ

dxµ
∮︂
γ

dyν∆µν(x− y) =

∫︂
k

∆µν(k)V
µ(γ, k)V ν(γ,−k) (4.3.10)

where the eikonal factor V µ is

V µ(γ, k) :=

∫︂
γ

dxµ e−ikx (4.3.11)

Then, the gauge part of (4.3.10) is proportional to kµV µ =
∫︁
γ
d(e−ikx), which vanishes for

a closed loop. Note that either of these arguments goes through even in the presence of
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a regulator, such as replacing 1
x2

→ µ2

(µ2x2)α
or shifting one of the integration contours via

γ → γ + ϵ. So this justifies the claim that we are allowed to simply use ∆µν =
δµν
x2

.

We begin with a circle geometry, x = (R cos θ,R sin θ). Then, dxµdyµ = R2 cos(θ −

θ′)dθdθ′ and so, in analytic regularization,

log⟨W (⃝)⟩ = −1

2

µ2R2

(2µ2R2)α

∫︂ 2π

0

dθ

∫︂ 2π

0

dθ′
cos(θ − θ′)

(1− cos(θ − θ′))α

= −1

2

µ2R2

(2µ2R2)α
2π

(︃
−2α+1π

Γ(1− 2α)

Γ(2− α)Γ(−α)

)︃ (4.3.12)

Taking α → 1 we find log⟨W ⟩ = π2, while α → d/2 − 1 leads to log⟨W ⟩ =

(µR)4−d 2π2Γ(3−d)
Γ(1−d/2)Γ(3−d/2) . This implies, for our large Nf QEDd problem, that10

log⟨W (⃝)⟩ =

⎧⎪⎪⎪⎨⎪⎪⎪⎩
4π2g

(4π)d/2Γ(d/2− 1)
R ≫ e2/(d−4)

e2R4−dπ
2−d/2Γ(3− d)Γ(d/2− 1)

2Γ(1− d/2)Γ(3− d/2)
R ≪ e2/(d−4)

(4.3.13)

For d < 4, which is the regime where the theory is UV free and has an interesting IR fixed

point, the log of the expectation value vanishes at short distances, implying that the UV

defect entropy is zero. On the other hand, the long-distance answer is positive. This is not

incompatible with the g-theorem [314], since here we are dealing with a bulk RG flow, not a

defect one.

As a check of the result above, we note that the α→ 1 limit of (4.3.12), when multiplied

by e2

4π2 , yields the well-known free Maxwell answer ⟨W (⃝)⟩ = exp(e2/4).

Furthermore, if we take d = 1 in (the first line of) the general expression (4.3.13), we find

log⟨W ⟩ = −2/Nf , while if we take d = 2 we find log⟨W ⟩ = 0. These agree with computations

performed directly in d = 1, 2.

We can reuse the results above to easily get the answer for general gauge group. Say we

take the Wilson line to be in a representation ρ of G; then, to tree level, the expectation

10The UV limit in d = 3 is special because R4−d becomes R, which is linear and hence a counterterm. In
this case one has to expand around α = d/2 − 1 and keep the subleading term as well. The result is the
usual R log(µR) behavior.
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value the loop is simply trρ[1] = dim(ρ). To next order we replace ∆µν → ∆µνδ
ab, where a, b

are adjoint indices, and we also take a trace over ρ. In other words, we replace

⟨aa⟩ → trρ[⟨aa⟩]

= trρ[t
atb]δab⟨aa⟩QED

= T (ρ) dim(G)⟨aa⟩QED

(4.3.14)

Therefore, the expectation value for non-abelian G reads

log(⟨Wρ(⃝)⟩/ dim(ρ)) = log⟨W (⃝)⟩QED × T (ρ) dim(G)

dim(ρ)T (R)
+O(N−2

f ) (4.3.15)

where T (R) arises because the effective coupling is gQCD = gQED × 1
T (R)

.

Again, if we take d = 1 we recover the answer derived independently in QCD1. If we take

d = 2, both answers vanish to order 1/Nf . In any case, the main conclusion is that (4.3.13)

admits a meaningful continuation to d ∈ C.

For future reference let us sketch the same result but in point-splitting regularization,

where we add a small shift to one of the integration contours. The easiest way to do this

is to push the second integration off the plane, so that x = (R cos θ,R sin θ, 0) and y =

(R cos θ′, R sin θ′, ϵ). This yields

−1

2

∫︂ 2π

0

dθ

∫︂ 2π

0

dθ′
R2 cos(θ − θ′)

2R2 − 2R2 cos(θ − θ′) + ϵ2
(4.3.16)

which evaluates to −π2R
|ϵ| + π2 +O(ϵ). The divergence is just − π

|ϵ| times the perimeter 2πR,

so it can be canceled by a local counterterm along the line. The finite part agrees with the

analytic computation from before.

A mild complaint for this regulator is that it requires a third direction, so it doesn’t

work if d < 3. It is in fact possible to point-split while keeping the two contours on the

same plane; the only way to do this, without having the contours intersect at all, is to

shrink one of them by a small amount. In other words, we take x = (R cos θ, R sin θ) and
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y = ((R + ϵ) cos θ′, (R + ϵ) sin θ′). Then,

log⟨W (⃝)⟩ = −1

2

∫︂∫︂ 2π

0

R(R + ϵ) cos(θ − θ′) dθ dθ′

(R sin θ − (R + ϵ) sin θ′)2 + (R cos θ − (R + ϵ) cos θ′)2

= −1

2
2π ×

⎧⎪⎨⎪⎩
2πR2

2Rϵ+ϵ2
ϵ > 0

−2π(R+ϵ)2

2Rϵ+ϵ2
ϵ < 0

= −π
2R

|ϵ|
+

⎧⎪⎨⎪⎩
1
2
π2 ϵ > 0

3
2
π2 ϵ < 0

+O(ϵ)

(4.3.17)

The singularity is −π2R
|ϵ| as before, but the finite part appears ambiguous: it depends on

whether we shrink the second contour or we expand it. This of course makes no sense, the

finite part should be scheme-independent. The resolution is that a local counterterm shifts

the expectation value by something proportional to the length of the line, but in this case

we have two lengths, 2πR and 2π(R + ϵ). So we split the difference and write the result as

− π
2|ϵ|×2π(R+ϵ/2)+π2+O(ϵ), where we once again read the finite, scheme-independent part

as π2. (Equivalently, we can also take the symmetric limit limϵ→0 = 1
2
(limϵ→0+ + limϵ→0−),

for the same answer).

As a final comment, we remark that we found the scheme-independent part of ⟨W ⟩ for

a circular geometry to be independent of the radius R. This is of course as expected, since

a circle has a single scale, and a conformal line has no scales of its own, and therefore there

is no dimensionless ratio the expectation value could depend on. Below we will consider a

rectangular geometry which has two scales, and we will find that ⟨W ⟩ is a non-trivial function

of their ratio. Another simple geometry with two scales is the ellipse, say with axes (a, b), for

which we find log⟨W ⟩ = −2πa
|ϵ| E(1− b2/a2)+ 1

2
π2(b/a+a/b)+O(ϵ), where E is the complete

elliptic integral of the second kind. The singularity is once again − π
2|ϵ| times the length of

the line, and the finite part π2(a/b+ b/a) is a non-trivial function of the dimensionless ratio

a/b. For a = b we recover the circle answer π2.

We now move on to the rectangular geometry that measures the potential energy between
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two probe charges:

(0, 0) (0, R)

(T, 0) (T,R)

(4.3.18)

We use both regularizations. We begin with y being the straight line between (0, 0) and

(T, 0), while x is the whole rectangle; we will then add the other pieces of the y path. We

parametrize y(τ ′) = (τ ′(T + 2ϵ)− ϵ,−ϵ), with τ ′ ∈ [0, 1], as well as

x(τ) =

⎧⎪⎪⎪⎪⎪⎪⎪⎪⎪⎨⎪⎪⎪⎪⎪⎪⎪⎪⎪⎩

(4τT, 0) 0 < τ < 1/4

(T, (4τ − 1)R) 1/4 < τ < 1/2

((−4τ + 3)T,R) 1/2 < τ < 3/4

(0, (−4τ + 4)R) 3/4 < τ < 1

(4.3.19)

Then, dxµdyµ = 4T (T +2ϵ)(Θ(0 < τ < 1/4)−Θ(1/2 < τ < 3/4))dτdτ ′ and so this segment

contributes

−2T 2

∫︂ 1/4

0

dτ

∫︂ 1

0

dτ ′
µ2

(µ2T 2(4τ − τ ′)2)α

+ 2T 2

∫︂ 3/4

1/2

dτ

∫︂ 1

0

dτ ′
µ2

(µ2(T 2(−4τ − τ ′ + 3)2 +R2)α

= µ2(1−α)
(︃
T 2R−2α

2F1(
1
2
, α; 3

2
;−T 2

R2 )

+
1

2(α− 1)

[︁
−R2(1−α) + (R2 + T 2)1−α + 1

1−2α
T 2(1−α)]︁)︃

= − 1

2(α− 1)
+ 1 +

T

R
arctan

T

R
+

1

2
log

µ2R2T 2

R2 + T 2
+O(α− 1)

(4.3.20)
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in analytic regularization, and

−2T (T+2ϵ)

∫︂ 1/4

0

dτ

∫︂ 1

0

dτ ′
1

(4τT − τ ′(T + 2ϵ) + ϵ)2 + ϵ2

+

∫︂ 3/4

1/2

dτ

∫︂ 1

0

dτ ′
1

(R + ϵ)2 + (T (4τ + τ ′ − 3) + 2τ ′ϵ− ϵ)2

= − πT

2|ϵ|
+
πT

4R
+ 1 +

1

2
log

T 2R2

2(T 2 +R2)ϵ2

+
T

2R
(arctan(T/R)− arctan(R/T )) +

⎧⎪⎨⎪⎩
−π/4 ϵ > 0

+3π/4 ϵ < 0

(4.3.21)

in point-splitting regularization.

Adding the other three segments amounts adding the same expression with T ↔ R, and

multiplying by 2, so all in all

log⟨W (□)⟩ = 2
T

R
arctan

T

R
+ log

µ2R2T 2

R2 + T 2
+ (R ↔ T ) (4.3.22)

for the analytic regularization approach, after absorbing the 1
2(α−1)

pole into a corner coun-

terterm. The point-splitting result, after removing the −π(T+R)
|ϵ| pole into a perimeter coun-

terterm, is in fact identical to this, thanks to standard arctan identities.

So both approaches yield the same answer, but they both introduce a dependence on the

arbitrary scale µ. This dependence is somewhat artificial in that the rescaling µ→ λµ can be

removed by a corner counterterm log(λ), so the result doesn’t depend on µ in a measurable

way. But at the same time it is not possible to remove this dependence, which means that

the configuration breaks the 1d scale invariance of the line (the more precise statement is

that this is a trace anomaly, see e.g. [315]). This is in fact the cusp anomalous dimension of

the line, as we elaborate on below.

Note that in analytic regularization, the circle and rectangle both had no need for a

perimeter counterterm. On the other hand, in point-splitting, the circle had a divergence

−π2R
|ϵ| , while the rectangle had a divergence −π(T+R)

|ϵ| ; these are both equal to − π
2|ϵ| × length,

so the same counterterm fixes both. This is of course as expected: for a fixed choice of

scheme, we should find the same counterterm for any geometry, since counterterms are local
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and thus do not care about the shape of the line. In other words, if two geometries have

different linear divergences, it would not be possible to fix both at the same time, and the

observable would be inconsistent. It is reassuring that the circle and rectangle lead to the

same counterterm, for both choices of regularization.

Note also that if we take the T ≫ R limit of the above, we find V (R) = −π/R+O(log T )

which, after multiplying by e2

4π2 , becomes V (R) = − e2

4πR
, which is the usual Coulomb potential

of free 4d Maxwell. On the other hand, for our large Nf QEDd problem,

V (R) = − 4πg

(4π)d/2Γ(d/2− 1)

1

R
R ≫ e2/(d−4) (4.3.23)

and therefore we learn that these theories are all Coulomb-like. This is of course the only

R dependence compatible with scale invariance, so this result is simply telling us that the

Wilson line is conformal.

We end this discussion with a quick analysis of the cusp, which we parametrize by two

segments x = (s, 0) and x = (s cosϕ, s sinϕ), where s ∈ (0,∞):

ϕ
(4.3.24)

We are more cavalier than before, and simply cutoff the s integral at short and long distances;

we find the same divergences as before, plus a new type, namely the cusp. This comes from

the crossed terms where x is horizontal and y is oblique:

−1

2
× 2×

∫︂ 0

∞
ds

∫︂ ∞

0

ds′
cosϕ

(s− s′ cosϕ)2 + (s′ sinϕ)2
− (same, with ϕ = π) (4.3.25)

where we subtract the ϕ = π term so that the cusp dimension of a straight line vanishes.

We interpret s and s′ as the proper times of the probe charges, and – as one often

does when using Schwinger’s parametrization – change variables into the “total proper time”

τ = s+ s′ ∈ (0,∞), and the “relative proper time” q = s
s+s′

∈ (0, 1). The Jacobian is simply

τ , so this integral simplifies to∫︂ L

ϵ

dτ

τ

∫︂ 1

0

dq
cosϕ

(q − (1− q) cosϕ)2 + (1− q)2 sin2 ϕ
− (· · · )

=
(︁
1 + 2 cot(ϕ) arctan(cot(ϕ/2))

)︁
log

L

ϵ

(4.3.26)
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whence Γcusp(ϕ) = −(1+2 cot(ϕ) arctan(cot(ϕ/2))) ≡ ([ϕ]−π) cot(ϕ−π)− 1, where [ϕ] = ϕ

mod 2π.

The rectangle has four cusps, each contributing a factor of

(︁
1 + 2 cot(ϕ) arctan(cot(ϕ/2))

)︁⃓⃓⃓⃓
ϕ=π/2

× logL ≡ + log(L) (4.3.27)

This is in agreement with our earlier computation (4.3.22), where we found · · ·+ 2 log(R2).

We note that the cusp dimension above satisfies Γcusp(ϕ) < 0,Γ′
cusp(ϕ) > 0,Γ′′

cusp(ϕ) < 0,

in agreement with the general analysis of [315]. For our QEDd problem, we are to multiply

this function by 4g
(4π)d/2Γ(d/2−1)

, which is positive for all 2 < d < 4, so these inequalities are still

satisfied. This is not entirely obvious, since [315] explicitly assumes unitarity, which is not

present in fractional d. Of course, the loss of unitarity does not show up in any of the simple

observables we look at in this paper, so it is not entirely surprising that our Γcusp(ϕ) behaves

as if the theory was unitary. Indeed, as pointed out at the beginning of this subsection, to

leading order in 1/Nf the photon propagator in QEDd has the same x dependence as the

propagator of 4d free Maxwell, which is of course unitary. So the only non-trivial statement

is that the coefficient that connects these two propagators is positive for all 2 < d < 4.

In any case, we note that 4g
(4π)d/2Γ(d/2−1)

is positive for 2 < d < 4, but actually vanishes

in d = 2, 4. For d = 4 this simply reflects the fact that the “infrared fixed point” of QED4

is essentially free. For d = 2, it is due to the fact that, while the Wilson line defines a

conformal defect for generic d, it becomes topological in d = 2: it becomes a Verlinde line of

SO(dimR)1/GT (R).

The factor 4g
(4π)d/2Γ(d/2−1)

becomes negative for d < 2, and the potential V (R) and the

cusp Γcusp(ϕ) become positive. While our general analysis should perhaps not be trusted all

that much below d < 2 (for example, does it even make sense to talk about the cusp angle ϕ

if we have fewer than two directions?), above we found that the d→ 1 limit of the general d

formulas does give the same answer as the direct d = 1 computation, so let us indulge. One

possible interpretation for the change of sign in 4g
(4π)d/2Γ(d/2−1)

is that this factor is actually
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the norm of the field strength fµν , namely

⟨∂[ρaµ](x)∂[σaν](0)⟩ = −g
∫︂
p

eipx
p[σδν][ρpµ]
pd−2

=
16g

(4π)d/2Γ(d/2− 1)

x[σδν][ρxµ]
x6

(4.3.28)

The fact that fµν has negative norm below d = 2 can be understood as the statement that this

field carries d− 2 degrees of freedom, this being the dimension of the vector representation

of SO(d−2) (which is itself the little group of massless, helicity 1 particles in d dimensions).

4.3.2 Quarks

In this subsection we sketch the computation of ⟨ψ̄(x)Wψ(0)⟩, with W is a straight Wilson

line connecting x to 0. We again are rather brief, as we shall encounter no surprises. By

conformal invariance, this correlation function is proportional to x−2∆(ψ) where, to tree level,

∆(0)(ψ) = (d− 1)/2. Below we compute the 1/Nf correction to this scaling dimension.

Our goal is to isolate the log divergence in this correlation function, from whose coefficient

we can read off ∆(1). The log divergence is associated with scale-less integrals, and we

introduce the notation

L :=

∫︂
k

1

kd
≡ 1

(4π)d/2Γ(d/2)
log(Λ2) (4.3.29)

for those.

For this geometry, the eikonal factor (cf. (4.3.10)) reads

V µ(x, k) =

∫︂ 0

x

dzµe−ikz = ixµ
1− e−ikx

kx
(4.3.30)

which, diagrammatically, we will denote as the insertion of an external source coupled to

the photon: ⊗ . Note that, unlike before, here kµV µ does not vanish, since the contour

is not closed; instead, kµV µ = i(1− e−ikx). This will cancel the gauge dependent part of the

undress correlator ⟨ψ̄(x)ψ(0)⟩.

There are three diagrams that contribute to this two-point function to leading order; we
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evaluate them in turn:

k

µ ν
= −

∫︂
pk

eipxS(p)γµS(p+ k)γνS(p)∆µν(k)

= ig

∫︂
p

eipxS(p)γµγα
[︃∫︂

k

pα + kα
kd−2(p+ k)2

(δµν + ξ
kµkν
k2

)

]︃
γνS(p)

= −g
[︃
(d− 2)2

d
+ ξ

]︃
S(x)L

(4.3.31)

Next,

⊗µ

ν
= −

∫︂
pk

eipxV µ(x,−k)S(p)γνS(p+ k)∆µν(k)

= g

∫︂
p

eipxS(p)γν
[︃∫︂

k

V µ(x,−k)S(p+ k)
1

kd−2
(δµν + ξ

kµkν
k2

)

]︃ (4.3.32)

We isolate the log divergence by focusing on the various degeneration limits. For this integral

there are two: p large with p+ k fixed, and the other way around. These are equal to each

other, so we consider one and multiply the answer by 2. For the remaining integral, we note

that, by Lorentz covariance, we can write∫︂
k

V µ(x,−k)S(k) 1

kd−2
(δµν + ξ

kµkν
k2

) = −i(γνf(x2) + xν/xg(x
2)) (4.3.33)

for some scalar functions f, g defined by

δανf(x
2) + xαxνg(x

2) =

∫︂
k

V µ(x,−k)kα
kd

(δµν + ξ
kµkν
k2

) (4.3.34)

Therefore, the diagram can be simplified into

= 2ig

∫︂
p

eipxS(p)

∫︂
k

V µ(x,−k)kµ
kd

(1 + ξ)

= 2g

∫︂
p

eipxS(p)

∫︂
k

(1− eikx)
1

kd
(1 + ξ)

= 2g(1 + ξ)S(x)L

(4.3.35)
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Finally, the last diagram contributing to this two-point function is

µ ν
⊗ ⊗

= −1

2
S(x)

∫︂
k

V µ(x,−k)V ν(x, k)∆µν(k)

= −1

2
gS(x)

∫︂
k

V µ(x,−k)V ν(x, k)
1

kd−2
(δµν + ξ

kµkν
k2

)

(4.3.36)

where 1/2 is a symmetry factor. The gauge part is straightforward, since kµV µ ∝ 1 − eikx,

which is easily integrated:∫︂
k

V µ(x,−k)V ν(x, k)
1

kd−2
ξ
kµkν
k2

= ξ

∫︂
k

(1− eikx)(1− e−ikx)
1

kd

= 2ξL

(4.3.37)

On the other hand, the physical part equals

−1

2
gS(x)

∫︂
k

x2

(kx)2
(1− eikx)(1− e−ikx)

1

kd−2
(4.3.38)

In order to evaluate this integral, we define

h(s) :=

∫︂
k

1

(kx)2
(1− eikxs)(1− e−ikxs)

1

kd−2
(4.3.39)

and note that the integral we are after is h(1). On the other hand, if we differentiate this

twice, we find

h′′(s) =

∫︂
k

(eikxs + e−ikxs)
1

kd−2
(4.3.40)

This is just (twice) the position-space scalar propagator, namely h′′(s) = 8
(4π)d/2Γ(d/2−1)

1
(sx)2

.

Therefore, integrating twice, we derive

h(s) = − 8 log(s)

x2(4π)d/2Γ(d/2− 1)
+ c1(x) + c2(x)s (4.3.41)

where c1, c2 are constants of integration. Furthermore, from the definition of h(s), it is clear

that a rescaling of s can be compensated by a rescaling of x, which means that log(s) must be

accompanied by 1
2
log(x2), with the same coefficient. Therefore, the physical part evaluates

to

−gS(x)((2− d)L +#Λ|x|) (4.3.42)
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where the second term comes from c2(x). This term, proportional to the length of the line,

is a perimeter counterterm, and we simply drop it. So, all in all, this diagram contributes

g(d− 2− ξ)S(x)L (4.3.43)

Adding up all contributions, we see that the ξ-dependent part nicely cancels, while the

physical parts add up to

gS(x)L × 4
d− 1

d
(4.3.44)

whence

∆(ψ) =
d− 1

2
− g

2(d− 1)

(4π)d/2Γ(d/2 + 1)
+O(g2) (4.3.45)

We can check this in various special cases. The anomalous dimension vanishes in d = 1,

it equals − 1
2Nf

in d = 2, − 32
3π2Nf

in d = 3, and vanishes in d = 4. The first three agree with

known low-dimensional results. The fourth simply says that our IR CFT becomes free in 4d

which, in a rough sense, corresponds to the logarithmic running e2 → 0 in QED4.

As another simple check, taking the trace of (4.3.44) gives the O(N0
f ) correction to the vev

⟨ψ̄ψ⟩. This is easily seen to vanish for all d, including d = 1, in agreement with ⟨ψ̄ψ⟩ = 1
2
Nf

being tree-level exact in d = 1.

Furthermore, the general d answer (4.3.45) also agrees with [316].

Finally, we describe the generalization to non-abelian gauge groups. The first change is

that the effective coupling becomes gQCD = gQED × 1
T (R)

. Furthermore, the gluon propagator

becomes ∆QCD = ∆QEDδ
ab, where a, b are color indices, and the vertex acquires a factor of

taR. This gives an extra factor of (tata)ij = T (R)dim(G)
dim(R)

δij. Thus the final result in QCD

is equal to the QED one multiplied by dim(G)
dim(R)

, in agreement with known results in integer

dimensions.

4.3.3 Mesons

In this subsection we study bilinear operators of the form ψ̄Γψ, where Γ is some matrix in

spinor-flavor space. In particular, we will be interested in the correlation function ⟨ψ̄Γψ ψ̄Γ̄ψ⟩
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where Γ, Γ̄ are in principle distinct matrices, assumed hermitian for concreteness. We begin

with G = U(1), and generalize to QCD afterwards.

To tree level this correlator is given by

⟨ψ̄Γψ(p) ψ̄Γ̄ψ(−p)⟩ = + (4.3.46)

The first diagram will show up quite often, so we give it a name: M(Γ, Γ̄). It evaluates

to
M(Γ, Γ̄) := −

∫︂
q

tr[S(q)ΓS(q + p)Γ̄]

=
1

g

1

2(d− 2)

tr[γαΓγβΓ̄]

tr[1]

−δαβp2 + (2− d)pαpβ
p4−d

(4.3.47)

In this notation, the second diagram is equal to

−M(Γ, γµ)∆µν(p)M(γν , Γ̄) (4.3.48)

We note that

M(Γ, γµ) =
1

g

1

tr[1]

tr[Γγµ]p2 − pµ tr[Γ/p]

p4−d
(4.3.49)

which vanishes when contracted with pµ, i.e., this structure is transverse. This implies that

the ξ-dependent part in M(Γ, γµ)∆µν(p) drops out, and the correlation function is gauge

invariant, as one would expect. So to summarize, to tree level this correlation function is

⟨ψ̄Γψ(p) ψ̄Γ̄ψ(−p)⟩ =M(Γ, Γ̄)− g

pd−2
M(Γ, γµ)M(γµ, Γ̄) (4.3.50)

Let us evaluate this explicitly for a few special cases. First, when Γ = γρ, the corre-

sponding bilinear is the gauge current ψ̄γρψ; for this, we find

⟨ψ̄γρψ ψ̄Γ̄ψ⟩ =M(γρ, Γ̄)− g

pd−2
M(γρ, γµ)M(γµ, Γ̄) (4.3.51)

which, using (4.3.49), becomes

=M(γρ, Γ̄)− δρµp2 − pµpρ

p2
M(γµ, Γ̄)

≡ 0

(4.3.52)
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Therefore, we learn that the correlation function ⟨ψ̄γρψ ψ̄Γ̄ψ⟩ vanishes for any choice of

Γ̄. This is in fact the expected result: the gauge current ψ̄γρψ is a null operator, since the

equations of motion imply
1

e2
∂µf

µν = ψ̄γνψ (4.3.53)

which becomes ψ̄γνψ ≡ 0 in the low energy limit e2 → ∞. (If we were to repeat the compu-

tation of ⟨ψ̄γρψ ψ̄Γ̄ψ⟩ using the full photon propagator e2δµν
p2(1−e2Π)

instead of the low energy one

− δµν
p2Π

, we would find that the correlator decays exponentially ⟨ψ̄γρψ(x)(· · · )⟩ ∼ exp(−µ|x|),

where µ ∼ (Nfe
2)1/(4−d) with e the short-distance dimensionful coupling. Therefore, the

gauge current creates the higher-d analogue of the Coleman-Schwinger boson; it defines a

massive operator and it decouples in the low energy effective theory).

Let us now consider Γ = Γ̄ = 1. Then, we find

⟨ψ̄ψ(p) ψ̄ψ(−p)⟩ =M(1, 1)− g

pd−2
M(1, γµ)M(γµ, 1) (4.3.54)

which, using (4.3.49), becomes

⟨ψ̄ψ(p) ψ̄ψ(−p)⟩ = −1

g

d− 1

d− 2

1

p2−d
− 1

g

1

tr[1]2
1

p4−d
(tr[γµ] tr[γ

µ]p2 − pµpν tr[γµ] tr[γν ]) (4.3.55)

From the p scaling we read off ∆(0) = d − 1, as expected. But we also encounter the

usual tr[γµ] issue. At this point we could just declare that only ∆(0) is meaningful, and

the overall coefficient is scheme-dependent anyway, so it doesn’t really matter if we fail to

analytically continue it. But in order to compute ∆(1) we will have to divide the O(g0) result

by this O(g−1) one, and therefore we cannot really sweep this issue under the rug. Perhaps

more importantly, unless we manage to simplify the factor pµpν into p2δµν , the expression

above seems to be in tension with Lorentz invariance, which requires the correlator of scalar

operators to be a function of p2 only.

The simplest way to deal with this awkward structure is to note that, for integer d, the

trace tr[γµ] is only non-zero when d = 1. But when d = 1, the two terms in tr[γµ] tr[γ
µ]p2 −

pµpν tr[γµ] tr[γν ] are actually equal to each other, and they cancel each other out. Therefore,

this structure vanishes for all d ∈ N, and the correct analytic continuation is that it vanishes

for all d ∈ C.
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If we insist that γµ must make sense at fractional d, then we can reach the same conclusion

via a more elaborate argument. In this case, we need the formal identity (4.2.22) (namely

tr[γρ]δµν = tr[γµ]δνρ = tr[γν ]δµρ). Contracting this identity with tr[γµ] yields tr[γρ] tr[γν ] =

tr[γµ] tr[γ
µ]δνρ, which again implies that the two terms tr[γµ] tr[γ

µ]p2 and pµpν tr[γµ] tr[γν ]

are equal to each other.

Whatever argument one likes best, the end result is very simple:

⟨ψ̄ψ(p) ψ̄ψ(−p)⟩ = −1

g

d− 1

d− 2

1

p2−d
(4.3.56)

Let us now consider the first non-trivial 1/Nf correction. This is given by the diagrams

+ +

+ +

+ +

(4.3.57)

We will call these three lines the “one-loop”, “two-loop”, and “three-loop” diagrams, re-

spectively (even though they are all of order O(N0
f )).

Our task is to isolate the log divergence in these Feynman integrals. In particular, logs

are associated with scale-less integrals, and we denote those by

L :=

∫︂
k

1

kd
≡ 1

(4π)d/2Γ(d/2)
log(Λ2) (4.3.58)

Let us go ahead and evaluate (4.3.57). The first and second one-loop diagrams are the

simplest: they are equal to each other, and also almost identical to the trace of (4.3.31).

Specifically, they both equal

−
∫︂
q

tr[(4.3.31)Γ̄S(q + p)Γ] = g

[︃
(d− 2)2

d
+ ξ

]︃
L

∫︂
q

tr[S(q)Γ̄S(q + p)Γ]

= −g
[︃
(d− 2)2

d
+ ξ

]︃
LM(Γ, Γ̄)

(4.3.59)
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The third one-loop diagram is also relatively straightforward: it equals∫︂
qk

tr[ΓS(q)γµS(q + k)Γ̄S(q + k + p)γνS(q + p)]∆µν(k) (4.3.60)

We can extract the log divergence by looking at the limit p→ 0; we can do this in two ways,

either we set S(q+k+p) → S(q+k) or S(q+p) → S(q). Adding up these two singularities,

we find
gL

d
M(γµγαΓ̄γαγµ,Γ) + gL ξM(Γ̄,Γ) + (Γ ↔ Γ̄) (4.3.61)

The one-loop diagrams, after cutting open the photon line, determine the tree-level value

of the four-point function ⟨aµ aν ψ̄Γψ ψ̄Γ̄ψ⟩. Therefore, they should be gauge invariant by

themselves. And indeed, adding up twice (4.3.59) (for the first two diagrams) plus (4.3.61)

(for the third), the ξ-dependent factors cancel out, as required.

Next, we evaluate the two-loop diagrams. As a useful first step, let us cut open the

photon lines and focus on the left half of these diagrams, i.e., let us compute the three-point

function ⟨aµ aν ψ̄Γψ⟩, as given by the diagrams

+ (4.3.62)

These evaluate to∫︂
q

tr[S(q + p)ΓS(q)γµS(q + k + p)γν ] +

⎛⎝ µ↔ ν

k ↔ −k − p

⎞⎠ (4.3.63)

This integral is given by some complicated function of the dimensionless ratio p2/k2; we will

consider the limit p2 ≪ k2, in which case we can evaluate the integral analytically:

= −2i

g

(d− 1)(d− 4)

d− 2

1

k4−d
tr[Γγ[µ/kγν]]

tr[1]
(1 +O(p2/k2)) (4.3.64)

Note that this vanishes when contracted with kµ, as required by gauge invariance. (We also

mention that, being a three-point function, the full p2/k2 dependence is determined from this

expression and the general constraints of conformal invariance; this dependence is somewhat

obscured in momentum space, and we will not need it anyway, so this limit p2 ≪ k2 is enough

for our purposes.)
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We can now evaluate the two-loop diagrams:∫︂
qkℓ

tr[S(q + p)ΓS(q)γµS(q + p+ k)γν ]

× tr[S(ℓ+ p)γσS(k + p+ ℓ)γρS(ℓ)Γ̄]

×∆µρ(k + p)∆νσ(k) + cross-channel

(4.3.65)

As before, we isolate the log divergence by looking at the limit p → 0; we can do this in

either of the first two lines. When we take p = 0, say, in the first line, we end up with the

same integral as in (4.3.64). Then, the fact that that integral is transverse means that these

two diagrams add up to something ξ-independent as well.

Plugging (4.3.64) into our two-loop integral, we find

− 2ig

tr[1]

(d− 1)(d− 4)

d− 2

∫︂
kℓ

tr[Γγ[µ/kγν]]

kd
tr[S(ℓ+ p)γνS(k + p+ ℓ)γµS(ℓ)Γ̄] + (Γ ↔ Γ̄)

(4.3.66)

The k integral is now elementary:

=
2gL

tr[1]

(d− 1)(d− 4)

d(d− 2)
(tr[Γγαγ[µγν]]− δµα tr[Γγν ] + δνα tr[Γγµ])∫︂

ℓ

tr[S(ℓ+ p)γνγαγµS(ℓ)Γ̄] + (Γ ↔ Γ̄)

(4.3.67)

which simplifies to

= −2gL

tr[1]

(d− 1)(d− 4)

d(d− 2)
tr[Γγαµν ]M(Γ̄, γαµν) + (Γ ↔ Γ̄) (4.3.68)

Finally, we evaluate the three-loop diagrams. These are actually the easiest: the left side

of these diagrams is identical to the two-loop diagrams we just computed, with Γ̄ → γρ, and

the right side of these diagrams is ∆ρσM(γσ, Γ̄). But the two-loop diagrams (4.3.68) are

easily seen to vanish when we replace Γ̄ → γρ, since both tr[Γ̄γαµν ] and M(Γ̄, γαµν) vanish

when we perform this replacement. Therefore, the three-loop diagrams are zero. (One can

reach this same conclusion from charge-conjugation symmetry.)

To summarize, the first non-trivial correction to the ⟨ψ̄Γψ ψ̄Γ̄ψ⟩ correlation function is

gL

d

(︃
−(d− 2)2M(Γ, Γ̄) +M(γµγαΓ̄γαγµ,Γ)

− 2

tr[1]

(d− 1)(d− 4)

(d− 2)
tr[Γγαµν ]M(Γ̄, γαµν)

)︃
+ (Γ ↔ Γ̄)

(4.3.69)
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As mentioned earlier, this should vanish if any of the insertions is a gauge current, i.e.,

if, say, Γ = γρ. And indeed, for this choice of Γ the first term is easily seen to cancel against

the second, while the third vanishes on its own.

Let us now take Γ = Γ̄ = 1. Then, we find

4(d− 1)gL

d

(︃
2M(1, 1) +

1

tr[1]

d− 4

d− 2
tr[γαµν ]M(1, γανµ)

)︃
= −4(d− 1)L

d

d− 1

d− 2

1

p2−d

(︃
2− d− 4

d− 2

tr[γαµν ] tr[γαµν ]

tr[1]2

)︃ (4.3.70)

Adding the tree-level result (4.3.56) to the one-loop result (4.3.70), we conclude that

⟨ψ̄ψ(p) ψ̄ψ(−p)⟩ ∝ 1 +
4(d− 1)gL

d

(︃
2− d− 4

d− 2

tr[γαµν ] tr[γαµν ]

tr[1]2

)︃
+O(g2) (4.3.71)

from where we read off ∆(1) as

∆(1)(ψ̄ψ) = − g

(4π)d/2Γ(d/2)

4(d− 1)

d

(︃
2− d− 4

d− 2

tr[γαµν ] tr[γαµν ]

tr[1]2

)︃
(4.3.72)

As a check, let us consider a few special cases of this. If d = 1, we get ∆(1) = 0. If d = 2,

we get ∆(1) = −1/Nf . If d = 3, we use tr[γαµν ] tr[γαµν ]

tr[1]2
= −3! to get ∆(1) = 128/3π2Nf . These

agree with known results in integer dimensions. If d = 4 we once again get ∆(1) = 0, as

expected.

Before we discuss the result above more thoroughly, let us quickly mention the non-abelian

case. As in previous subsections, all diagrams considered here stay the same, and we just

multiply by the usual color factor dim(G)/ dim(R). The only exception is that the gluonic

line in (4.3.46) acquires corrections due to ghosts and self-interactions, which contribute

to order O(N0
f ). But as we argued below (4.3.55), this diagram does not contribute to

ψ̄ψ, so this does not affect our analysis above. Taking our QED result and multiplying by

dim(G)/ dim(R) matches the d = 1, 2, 3 expectations.

How should we think of (4.3.72) at fractional d? If we believe equation (4.2.23) for

fractional d, and thus also its implication that (d− 3) tr[γαµν ] ≡ 0, then we would conclude

that the second term is exactly zero for all d ̸= 3, and this scaling dimension is discontinuous

there.
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This conclusion is not actually precise enough. The correct interpretation of (4.3.72) for

d ∈ C requires us to think about (a regularized version of) Rep(Pin(∞)) more carefully.

Before we do that, we would like to mention the more naive approach which, while ultimately

not well-defined, yields some amusing results.

For the naive approach, we assume that γµ makes sense for d ∈ C, and that its various

traces are non-zero, analytic functions of d. If this is the case, we must reckon with the

extraneous operators in (4.2.24); these are formally scalars, and have the same tree-level

scaling dimension as ψ̄ψ, and therefore we must solve a (infinite-dimensional) degenerate

perturbation theory problem. We don’t think this is the correct perspective, and therefore

we won’t dwell on this too much. But as an illustration, let us truncate the extraneous

operators to the subset {ψ̄ψ, tr[γρστ ]ψ̄γρστψ}. Now, take the general formula (4.3.69) and

plug in Γ = Γ̄ = 1 + χ tr[γρστ ]γ
ρστ for some coefficient χ, to be chosen below. Then, one

finds

⟨ψ̄Γψ(p) ψ̄Γ̄ψ(−p)⟩ =M(Γ, Γ̄)− 4gL

d

(︃
(d− 4)

{︃
4 +

χ−1 − 6 tr[1]

tr[1]

d− 1

d− 2

}︃
M(Γ̄,Γ)

−
{︃
6(d− 3) +

χ−1 − 6 tr[1]

tr[1]

(d− 1)(d− 4)

(d− 2)

}︃
M(1,Γ)

)︃ (4.3.73)

The point of (4.3.73) is the following: if we choose the coefficient χ such that the term

proportional to M(1,Γ) vanishes, namely

χ−1 ≡ − 12

(d− 4)(d− 1)
tr[1] (4.3.74)

then the two-point function becomes

⟨ψ̄Γψ(p) ψ̄Γ̄ψ(−p)⟩ =M(Γ, Γ̄)

(︃
1 +

8(d− 1)gL

d
+O(g2)

)︃
(4.3.75)

from which we can read off ∆(1) as

∆(1)
(︁
ψ̄(1 + χ tr[γρστ ]γ

ρστ )ψ
)︁
= − 8(d− 1)g

d(4π)d/2Γ(d/2)
(4.3.76)

This is now analytic in d. But if we take d = 3, we get −64/3π2Nf , instead of the correct

answer 128/3π2Nf . The reason for this is that, if we take d = 3, the operator in parentheses
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in (4.3.76) actually vanishes. Indeed, in d = 3 one has tr[γρστ ]γ
ρστ = −6 tr[1], and therefore(︃

− 12

(d− 4)(d− 1)
tr[1]

)︃−1

tr[γρστ ]γ
ρστ d→3−−→ −1 (4.3.77)

So in this approach, we would conclude that we either work with the operator ψ̄ψ, whose

scaling dimension is discontinuous at d = 3, or with an operator ψ̄(1+χ tr[γρστ ]γρστ )ψ whose

dimension is analytic in d, but the operator itself is discontinuous, and it becomes null at

d = 3. Furthermore, there is no scalar operator in QED3 with dimension −64/3π2Nf , so the

formula (4.3.76) does not match anything in the physical theory11. This is reminiscent of

various results in the literature, where one observes that continuous families of CFTs, when

particularized to concrete values of the parameter, appear to contain operators that are not

present if one began with that choice of the parameter, see e.g. [223, 226, 227] for recent

examples.

We now explain what we believe is a more fruitful perspective – this being that one should

be working in “Rep(Pin(∞))”. In short, we will try to work with stable quantities, namely

we will ignore low d exceptions and only use formulas that are correct for all sufficiently

large d ∈ N. In particular, all traces over the even part of the Clifford algebra are stable,

while the traces over the odd part will be replaced by their stable limit, i.e., they will be

declared to be zero. This last prescription is correct at large enough d, but wrong at small

d ∈ N, and therefore we will have to fix the low rank exceptions by hand, in a systematic

way.

Note that declaring that odd traces are zero is formally equivalent, as we did in the

discussion of ψ̄(1+χ tr[γµνσ]γµνσ)ψ, to adding suitable extraneous operators with coefficients

chosen so that these traces cancel out. The notion of a direct limit makes this precise.

In any event, once we declare that all traces with an odd number of gammas vanish, we

11Intriguingly, there is one bilinear in QED3 with this scaling dimension: the adjoint scalar ψ̄iψ
j − trace,

which has ∆(1) = −64/3π2 [317, 318]. This is not a flavor singlet, so this operator is distinct from our ψ̄ψ.
It is not clear to us if this is just a coincidence, but we do mention that, as explained around (4.2.20), the
notion of flavor quantum numbers is somewhat ambiguous in fractional dimension, so it is conceivable that
the singlet and the adjoint get mixed up somehow. It would be interesting to study the interplay between
flavor symmetries and analytic continuation of d more carefully in the future.
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can easily write down expressions for scaling dimensions that are analytic in d. The issue is

that these formulas will yield the wrong answer for small d, as these expressions are missing

the contribution of these traces that we set to zero by hand. The obvious question is whether

we can harmonize the two approaches and write down observables that are both analytic in

d and correct for all d ∈ N, and not just for large enough d.

A hint toward realizing this goal is to notice that ψ̄γµ1···µnψ is a rank-n anti-symmetric

tensor only generically, but not always. For example, ψ̄γµ1µ2µ3ψ is actually a scalar when

d = 3. More generally, the low-rank exceptions where tr[γµ1···µn ] is non-zero are precisely the

situations where these fermion bilinars are actually scalars.

This means that if we want to understand the scalar operator ψ̄ψ at low d, we must also

consider the higher-rank forms ψ̄γµ1···µnψ as well, since the latter are sometimes scalars too.

In a formal sense, in fractional d we must allow for something like mixing of Lorentz tensors

of different spin, since at exceptional values of d, these representations become isomorphic.

So, with this insight in mind, let us compute ∆(ψ̄γµ1···µnψ) to leading order in 1/Nf . For

this we can just reuse our general formulas (4.3.50), (4.3.69) and simply plug in Γ = Γ̄ =

γµ1···µn . For generic d these formulas will involve, much like in the case of ψ̄ψ, traces of

an odd number of gammas. The stable limit of these dimensions is easily worked out, the

answer being ˆ︁∆(ψ̄ψ) = 1− 8(d− 1)

d

g

(4π)d/2Γ(d/2)ˆ︁∆(ψ̄γµψ) = 0

ˆ︁∆(ψ̄γµ1µ2ψ) = 1 +
8(d− 3)

d

g

(4π)d/2Γ(d/2)ˆ︁∆(ψ̄γµ1µ2µ3ψ) = 1− 8(d− 4)(d+ 1)

d(d− 2)

g

(4π)d/2Γ(d/2)

(4.3.78)

etc. Here, the hat means that this scaling dimension refers to the direct limit d → ∞, i.e.,

these expressions are only correct for large enough d, and they fail at small d ∈ N, since

they ignore traces that are actually non-zero sometimes. The vanishing of ˆ︁∆(ψ̄γµψ) simply

reflects the fact that this bilinear is the gauge current and hence a null operator. We will

forget about this bilinear from now on.
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As a quick check of the result above note that, if we take d = 4− 2ϵ and expand at small

ϵ, we find

ˆ︁∆(ψ̄ψ) = 3− 2ϵ+
1

tr[1]

(︃
−18ϵ+ 15ϵ2 + 35

2
ϵ3 + (83

4
− 36ζ(3))ϵ4 + · · ·

)︃
ˆ︁∆(ψ̄γµ1µ2ψ) = 3− 2ϵ+

1

tr[1]

(︃
6ϵ− 13ϵ2 − 9

2
ϵ3 + (7

4
+ 12ζ(3))ϵ4 + · · ·

)︃
ˆ︁∆(ψ̄γµ1µ2µ3ψ) = 3− 2ϵ+

1

tr[1]

(︃
30ϵ2 + 13ϵ3 − 35

2
ϵ4 + · · ·

)︃ (4.3.79)

in perfect agreement with the corresponding ϵ expansion. The reason these two computations

match is that the ϵ expansion of [309] uses the ’t Hooft-Veltman prescription that is adapted

to a neighborhood of d = 4, in which traces with an odd number of gammas do vanish.

The key point of (4.3.78) is the following. If we take ˆ︁∆(ψ̄ψ) and plug in d = 3, we

find 1− 64
3π2Nf

, which differs from the correct answer as computed directly in d = 3, namely

1 + 128
3π2Nf

. On the other hand, in d = 3 the operator ψ̄γµ1µ2µ3ψ is a scalar and, if we takeˆ︁∆(ψ̄γµ1µ2µ3ψ) and plug in d = 3, we do get the correct answer, i.e., 1 + 128
3π2Nf

. That being

said, the formula for ˆ︁∆(ψ̄γµ1µ2µ3ψ) gives the wrong answer for d = 2, while the formula

for ˆ︁∆(ψ̄ψ) gives the correct answer in this dimension. So neither ˆ︁∆(ψ̄ψ) nor ˆ︁∆(ψ̄γµ1µ2µ3ψ)

matches the honest ∆(ψ̄ψ) for all d ∈ N, but they do each give the correct answer for some

specific d ∈ N. The graph on page 107 plots the functions (4.3.78).

To leading order in 1/Nf the operator ψ̄ψ only picks up the trace tr[γµ1µ2µ3 ], which is why

we find one extra branch adapted to d = 3. To higher orders in 1/Nf one finds higher odd

traces tr[γµ1···µn ], and therefore there are infinitely many branches for ∆(ψ̄ψ), each adapted to

a neighborhood of a given odd d. The analytic continuation of d for a generic QFT does not

live on C, but rather on some infinite cover thereof; only on such cover are observables truly

analytic. It would be interesting to try and make this statement mathematically rigorous,

especially in relation to analytic continuation of other discrete parameters, like the number

of colors in large Nc gauge theories.

An important aspect that should be considered more carefully is that the factor of
g

(4π)d/2Γ(d/2)
in (4.3.78) is ∼ 2d

tr[1]
sin(πd/2)O(1/

√
d) at large d. This grows with d and there-

fore the ∆(1) correction is larger than the tree-level result ∆(0) for sufficiently large d, and
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the large-Nf expansion breaks down. In other words, our result for ∆(ψ̄ψ) is only reliable

in the limit 2⌊d/2⌋Nf ≫ 2d. This puts any notion of uniqueness into question since, as we

argued, analytic continuation can only possibly be unique if we impose “nice behavior” at

d→ ∞. For fixed Nf , the inequality 2⌊d/2⌋Nf ≫ 2d is always disobeyed for sufficiently large

d, and therefore it is impossible to establish whether our result is unique or not. It appears

to us that, ultimately, the topic of uniqueness in analytic continuation of QFTs can only be

addressed in non-perturbative settings.

4.4 QEDd Gross–Neveu–Yukawa model at large Nf

We now add a Gross–Neveu–Yukawa interaction to large-Nf QEDd, as studied in the previous

section. The purpose is to understand how the branch structure discussed above is modified

by the additional interaction. We consider the Euclidean action [319, 320]

L =

Nf∑︂
i=1

[︁
−ψ̄iγµ(∂µ + iAµ)ψi + ϕ ψ̄iψi

]︁
+

1

4e2
F 2
µν +

Nf

2u2
(∂µϕ)

2 +Nfλ
2
0ϕ

4 (4.4.1)

and take the large-Nf limit with e2Nf , u, and λ0 held fixed.

The scalar field is normalized so that its bare propagator is

Gbare
ϕ (p) =

u2

Nfp2
(4.4.2)

At large Nf , the leading correction to the scalar two-point function comes from the fermion

bubble

Σ(p) =

∫︂
ℓ

tr

[︄
/p+ /ℓ

(p+ l)2
/ℓ

ℓ2

]︄
= −1

2
tr[1]κd(1, 1)|p|d−2 (4.4.3)

In d = 3, this gives Σ(p) = −Nf |p|/8 when tr[1] = 2Nf . The effective scalar propagator is

therefore
Geff
ϕ (p) =

[︂(︁
Gbare
ϕ (p)

)︁−1 − Σ(p)
]︂−1

=

[︃
Nfp

2

u2
+

1

2
tr[1]κd(1, 1)|p|d−2

]︃−1 (4.4.4)

For 2 < d < 4, the fermion bubble dominates in the infrared, and hence

Gϕ(p) =
h

|p|d−2
+ · · · , h :=

2

tr[1]κd(1, 1)
(4.4.5)
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Here, the dots denote corrections subleading in the large-Nf infrared expansion. Thus, in

the infrared, the effective scalar propagator has the same large-Nf scaling as the gauge-field

propagator.

The Feynman rules relevant for the leading 1/Nf computation are

= S(p) = −i /
p

p2

µ ν
= ∆µν(p) =

g

pd−2

(︃
δµν + ξ

pµpν

p2

)︃
= G(p) =

h

pd−2

(4.4.6)

where g is the same effective coupling as defined in (4.3.3). The gauge and scalar vertices

are12

µ
= −iγµ, = 1 (4.4.7)

4.4.1 Fermion bilinears

We now consider bilinears ψ̄Γψ and use the notation M(Γ, Γ̄) of Sec. 4.3 for the correspond-

ing fermion bubble. At leading order, the connected two-point function receives one new

contribution, namely scalar exchange. Thus, the connected two-point function is given by

⟨ψ̄Γψ(p) ψ̄Γ̄ψ(−p)⟩ = + + (4.4.8)

which combine to give

⟨ψ̄Γψ(p) ψ̄Γ̄ψ(−p)⟩tree =M(Γ, Γ̄)− g

pd−2
M(Γ, γµ)M(γµ, Γ̄) +

h

pd−2
M(Γ, 1)M(1, Γ̄) (4.4.9)

As before, M(Γ, γµ) is transverse, so the ξ-dependent part of the photon propagator drops

out.

For the scalar bilinear Γ = Γ̄ = 1, one has

M(1, 1) = −1

2
tr[1]κd(1, 1)|p|d−2, M(1, γµ) = 0. (4.4.10)

12The quartic interaction is irrelevant for d < 4, and we will not include it in the leading large-Nf analysis.
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The first and the third terms in (4.4.8) therefore cancel,

⟨ψ̄ψ(p) ψ̄ψ(−p)⟩tree = 0 (4.4.11)

Thus, the leading connected correlator of the scalar bilinear vanishes. This is just the

statement that, at the critical point, the inverse effective scalar propagator is generated by

the same fermion bubble that appears in M(1, 1).

In what follows, this vanishing connected correlator will not be used as the starting point

for extracting an anomalous dimension. Rather, to compare with the pure QED result for

Γ = Γ̄ = 1, we focus on the logarithmic corrections to the one-particle-irreducible bilinear

two-point function, namely the fermion bubble.13

At the next order in the large-Nf expansion, the logarithmic correction to the 1PI bi-

linear two-point function receives contributions from three classes of diagrams: pure gauge-

exchange diagrams, pure scalar-exchange diagrams, and mixed gauge-scalar diagrams. The

pure gauge-exchange contribution is the same as in the pure QEDd calculation above. We

discuss the last two classes in turn.

We first consider the scalar-exchange contribution to the logarithmic part of the 1PI

bilinear two-point function. Equivalently, this is the Gross–Neveu–Yukawa part of the cal-

culation with the gauge field turned off. The relevant diagrams are the scalar analogues of

the diagrams considered in pure QEDd

+ + + + (4.4.12)

The first two diagrams are self-energy insertions on the fermion lines, the third diagram is

the vertex correction, and the last two diagrams contain two scalar exchanges. Similarly,

the logarithmic terms can be extracted using the same momentum-region argument as in

the pure QEDd calculation. Keeping only the relevant large momentum regions gives the

logarithmic contribution to the 1PI bilinear two-point function.

13Since the leading connected correlator in this channel vanishes after scalar exchange is included, the L
term in the 1PI bubble is not a correction to a nonzero leading two-point function of ψ̄ψ. Therefore, the
usual extraction of an anomalous dimension from a logarithmic correction to a two-point function does not
directly apply.
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The scalar correction to the fermion propagator gives∫︂
k

S(p)S(k + p)S(p)G(k) = −hd− 2

d
L S(p) (4.4.13)

Thus, the first two diagrams contribute

−2h
d− 2

d
L M(Γ, Γ̄) (4.4.14)

The third diagram gives

−h
d
L M(Γ, γαΓ̄γα) + (Γ ↔ Γ̄) (4.4.15)

The logarithmic contributions from the last two diagrams cancel. The scalar contribution

to the logarithmic correction is therefore(︃
−hd− 2

d
L M(Γ, Γ̄)− h

d
L M(Γ, γαΓ̄γα)

)︃
+ (Γ ↔ Γ̄) (4.4.16)

For the scalar bilinear Γ = Γ̄ = 1, this becomes

−4h(d− 1)

d
L M(1, 1) (4.4.17)

There are also mixed diagrams, with one gauge exchange and one scalar exchange

+ + + (4.4.18)

For general bilinear insertions Γ and Γ̄, the mixed diagrams are gauge invariant by themselves.

Indeed, the ξ-dependent part of the photon propagator is proportional to

kµkα [M(Γ, γµγα)−M(Γ, γαγµ)] (4.4.19)

which vanishes. We may therefore keep only the transverse part of the photon propagator.

After extracting the logarithmic contribution, the mixed diagrams give

Mmix =
4(d− 3)gh κd(1, 1)L

d
M(Γ, γµα) tr[Γ̄γαµ] + (Γ ↔ Γ̄) (4.4.20)

For Γ = Γ̄ = 1, this term vanishes by using tr[γαµ] = 0. Thus, the mixed diagrams do not

contribute to the scalar bilinear at this order.
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The gauge contribution is the same one found in the pure QEDd calculation. Combining

the scalar, gauge, and mixed contributions, the logarithmic correction to the 1PI bilinear

two-point function is(︃
−hd− 2

d
L M(Γ, Γ̄)− h

d
L M(Γ, γαΓ̄γα)

)︃
+
gL

d

(︃
−(d− 2)2M(Γ, Γ̄) +M(γµγαΓ̄γαγµ,Γ)

− 2

tr[1]

(d− 1)(d− 4)

d− 2
tr[Γγαµν ]M(Γ̄, γαµν)

)︃
+

4(d− 3)gh κd(1, 1)L

d
M(Γ, γµα) tr[Γ̄γαµ] + (Γ ↔ Γ̄).

(4.4.21)

This formula is the QEDd–GNY analogue of the logarithmic 1PI meson result in the pure

gauge theory.

For the scalar bilinear Γ = Γ̄ = 1, the mixed term vanishes, and one finds

M(1, 1)L

[︃
−4h(d− 1)

d
+

4g(d− 1)

d

(︃
2− d− 4

d− 2

tr (γαµν) tr (γαµν)

tr(1)2

)︃]︃
(4.4.22)

Thus, the scalar channel in the QEDd–GNY model inherits the same low-rank obstruction

as in pure QEDd. For generic d the odd trace is absent in the stable limit, while at d = 3 it

is nonzero and changes the logarithmic coefficient. The Yukawa interaction shifts the scalar

part of the 1PI correction, but it does not remove the branch structure associated with the

exceptional identity γµνρ ∼ ϵµνρ in three dimensions.

We close with a caution about the interpretation of this result. The combination of a

vanishing leading connected correlator and a nonzero logarithm in the 1PI kernel may look

like a logarithmic CFT. This is not the right conclusion yet. In the GNY theory, ψ̄ψ belongs

to a scalar-singlet sector containing operators such as ϕ, ϕ3, and ∂2ϕ. These operators are not

all independent, since the scalar equation of motion relates them. Thus, the correct question

is not whether the single object ψ̄ψ has a logarithmic two-point function. One must first

quotient by the equation-of-motion relation and then separate descendant directions from

primary directions. Only on this reduced space of independent scalar primaries does it make

sense to ask whether the dilatation operator is diagonalizable, or instead has a Jordan block.

We will not carry out this operator-mixing problem here.
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4.5 Conclusions and future directions

In this paper we have argued that analytic continuation in the number of spacetime dimen-

sions d is a meaningful operation, but one that is also remarkably subtle.

We showed that, if we think of d as living in C, then correlation functions, OPEs, and

scaling dimensions of generic operators are all discontinuous, even in theories as simple as

the free fermion CFT. On the other hand, we provided evidence that analyticity is recovered

if we consider some infinite cover of C, although this last perspective definitely warrants a

much more thorough study.

A simple application of our results is the following. The QCD theory we studied in

section 4.3 is known to be dual to a WZW model when d = 2 (see e.g. [321]). Then,

the analytic continuation in d we constructed can be interpreted as one specific choice for

analytic continuation of this 2d theory (see e.g. [322, 323] for somewhat recent efforts for

such problem). The rank of the WZW model is Nf , so we only have a continuation for

large rank. The question of how to construct a non-perturbative continuation is still open,

of course.

As stressed in the introduction, analytic continuation in d requires a choice of target for

all d ∈ N, i.e., it is not an operation that is intrinsically defined for a QFT that lives in

one specific d. That being said, some families might not have a meaningful continuation if

we insist on having a target for all d ∈ N, but the continuation might exist if we content

ourselves with having a target for some congruence class in N. As a simple illustration, the

integer sequence an = (−1)n does not have a nice continuation to the complex n ∈ C plane,

but if we unzip N into the even and odd integers, then we do get two healthy continuations,

namely an = 1 and an = −1. In this sense, it might be the case that some QFT that is

naturally defined for d = 3 might fail to have a nice continuation if we insist that we want all

d ∈ N, but the continuation might be well-defined if we only require a target at d ∈ 2N+ 1.

For example, because of Bott periodicity, fermions might have a nicer continuation in d

if we consider the eight cases d ∈ 8N+ k, k ∈ {0, . . . , 7} separately. This would allow us, for
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example, to analytically continue Majorana fermions.

An interesting family of QFTs one might want to analytically continue in d is Chern-

Simons(-matter) theories. In the same way we set up the analytic continuation of QED/QCD

via the 1/Nf expansion, in CS one can perform a 1/k expansion, which one could use to try

and define a continuation perturbatively. This continuation in d should present all the same

subtleties we explored here14, and likely many more. As before, defining this continuation

requires a choice of target for an infinite family of d ∈ N; here one natural choice is to take

the d-dimensional Chern-Simons form for all d ∈ 2N+ 1.

Although we do not have anything sharp to say about this, it should be useful to think

about the complications induced by tr[γµ1···µn ] in the language of von Neumann algebras.

Indeed, if Pin(d) for fractional d is morally Pin(∞), then we should perhaps think of the

γµ’s for fractional d as operators acting on some infinite-dimensional space, and their trace

should be regularized somehow (while preserving all the properties required by QFT, namely

Lorentz invariance, linearity and cyclicity). Looking at our various expressions for ∆(ψ̄ψ),

we see that observables always depend on these traces via the quotient tr[γµ1···µn ]/ tr[1], i.e.,

these are indeed regularized traces, if only formally.

Another aspect that invites further analysis is the connection between analytic continua-

tion of d and of N . One simple remark in this context is that the difficulty in defining traces

of γµ in fractional d can be reformulated entirely in the language of analytic continuation of

flavor symmetries. Indeed, the gamma matrices can equivalently be thought of as Majorana

fermions in an auxiliary 0+1d system, in terms of which tr[γµγν · · · ] = ⟨ΨµΨν · · · ⟩.15 As far

14As we mentioned before, generic operators in a chiral theory should behave similarly to parity-odd
operators in a vector-like theory. For example, we saw that in regular QCD the parity-odd operator ψ̄ψ
was rather subtle at fractional d, but the gauge sector (Wilson lines) were perfectly well-behaved. Once
we give up reflection symmetry, the gauge sector should become subtle as well. For instance, without
this symmetry, the most general photon two-point function compatible with gauge invariance is Πµν(p) =
(p2δµν − pµpν)Π

even(p2) + ipσ tr[γµνσ]Π
odd(p2). Therefore, if CS theories admit continuation in d at all, the

gauge sector will acquire a branched structure in d similar to the one in ψ̄ψ discussed in this paper.

15The fact that tr[γµ1···µn ] is non-zero only when n = d has a simple interpretation in this language: the
correlation function vanishes due to the d Ramond zero-modes, unless we insert the same number of Ψ’s.
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as these Majorana fermions is concerned, the group Pin(d) is a flavor symmetry.16

Let us also emphasize that the obstructions to analyticity in d or N are always due

to low rank exceptions. Indeed, the direct limit of a representation is always analytic,

by construction, since this limit is defined by considering only the asymptotic behavior in

d,N → ∞, which is smooth. In this sense, the non-analyticity reflects features that are

non-perturbative in 1/d or 1/N . It would be nice to understand this better, specifically

by drawing insights developed in the context of large Nc gauge theories. (There, unstable

representations are usually called “heavy” or “large”.)

Let us finally go back to one of the original motivations we mentioned in the introduc-

tion, namely dim-reg in the context of supersymmetry. Our main conclusion is that analytic

continuation in d is very subtle; therefore, if we only care about this operation as a sim-

plifying device for loop computations, then we have nothing to offer: the rigorous way to

analytically continue requires more work than dim-reg saves. Conversely, if one is interested

in this continuation for its own sake (e.g., can we find an interpolation between d = 3 and

d = 4 Seiberg-like dualities?), then unfortunately we also have reasons to be pessimistic:

supersymmetry itself is, in a sense, a low d exception. It is not clear to us how to set up a

healthy SUSY target for all d ∈ N. We leave this possibility open for now.

16More precisely, the flavor symmetry is O(d); the double-cover Pin(d) appears because the vacua of
these fermions realize the symmetry projectively. This is just the statement that this flavor symmetry has
a ’t Hooft anomaly. Note that the correlation functions of Ψµ present unstable behavior even though this
operator transforms under the vector representation of O(d), which is stable; this happens because the
ground state of the theory is itself unstable.
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